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Abstract

In this Thesis, we will work at the interface between particle physics and
gravity.

At first we will discuss a broad class of possible extensions of General
Relativity, namely Metric-Affine Gravity. In general, this kind of theo-
ries predict the existence of a large number of new degrees of freedom,
which in general could be pathological. In fact, for general values of
the coupling in the Lagrangian, these new states could be tachyons or
ghosts. Our aim will be the construction of prototypical metric-affine
theories which are healthy and “simple”, in the sense that they contain
only a new propagating particle on top of the graviton.

The second issue that we will investigate is the cosmological constant
problem. We will see that computing the back-reaction of quantum
fields on the spacetime in a self-consistent way combined with the use
of a dimensionless cutoff results in a radically different prediction with
respect to the usual one: the spacetime tends to become flat in the limit
in which the cutoff goes to infinity.
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Chapter 1

Introduction

Among all the fundamentals interaction known to us, gravity is the one of which
we have the most direct and immediate experience: since the dawn of mankind we
have felt our own weight and seen apples falling from trees. Things that are heavy
move downwards. All pretty straightforward. Then Newton came and with him the
discovery that gravity was a bit more complicated and that its laws explained not
only the motion of bodies on the Earth, but also the motion of the Heavens (namely,
the motion of the planets). Then Einstein came, and things become even more
complicated both mathematically (with the prominent role played by differential
geometry and tensors) and conceptually (with mind-bending concepts such as black
holes and the possibility of an expanding universe). Although the list of successes
of General Relativity (GR) is fairly long, there are still some unresolved questions.
Some of these are directly related to observations, such as the nature of dark matter
and dark energy. Others are more conceptual and stem from the fact that in the end
we would like to reconcile GR with particle physics, i.e. with quantum field theory
(QFT). However, when one tries to perform this feat, several problems arise. Let us
just consider two of them and two possible solutions. The first problem is that, at
first glance, the usual Einstein-Hilbert Lagrangian is quite different from the Yang-
Mills one so familiar to particle physicists. This discrepancy can be ameliorated in
the framework on Metric-Affine Gravity (MAG): assuming that the affine connection
is a dynamical object the theory can be rewritten in a way that resembles much more
the theories of the other fundamental interactions. Then the question becomes to
determine which are the propagating degrees of freedom of the theory and which are
their properties. This will be one of the themes that we will explore in the following.
The second problem is that the blind application of the usual techniques of quantum
field theory in the computation of the vacuum energy of fields leads to the infamous
cosmological constant problem: the prediction of a large cosmological constant, in
spite of the tiny value that is actually measured by astronomers. A possible solution,
as we will see, consists in using a different type of cutoff for regularizing divergences
and in the strategic use of the equations of motion for going on-shell in a self-
consistent way. We will discover that this procedure can produce quite surprising
results. From a technical point of view, this Thesis is organized as follows:

• In Chapter 2 we will give an introduction to MAG theories. After properly
defining the various objects on interest, we will adopt an effective field theory
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(EFT) perspective and address the question of the construction on the most
general Lagrangian containing terms up to mass-dimension four. Then we
will introduce the spin projector formalism, which will allow us to study the
propagation properties of the various degrees of freedom of the theory. This
Chapter is based on [1, 2] and does not contain original material.

• In Chapter 3 we will specialize to antisymmetric MAG theories (gravitational
theories with torsion, but with metric-compatible connection), and we will
address the problem of constructing what we call ”simple” MAGs, namely
theories propagating only the graviton and one other healthy particle (i.e. a
particle that is not a tachyon nor a ghost). This Chapter is based on [3].

• In Chapter 4 we will deal with the cosmological constant problem. Working in
a Euclidean setting, we will study what happens when the back-reaction on the
spacetime of quantum fields coupled to gravity is computed in a self consistent
way, using a dimensionless cutoff to regularize the theory. The surprising
result is that when the cutoff is sent to infinity the spacetime becomes flat,
a conclusion at odds with the typical lore of quantum field theory in curved
spacetime. This Chapter is based on [4].

• Finally, in Chapter 5 we will recapitulate the main results and point towards
some possible future directions.

4



Chapter 2

Introduction to Metric-Affine
theories of gravity

Einstein’s General Relativity is one of the most successful theories in the history
of physics, but it is unlikely to be the definitive theory of the gravitational inter-
action. In the literature several possible alternatives and extensions of GR have
been discussed, such as scalar-tensor theories [5], higher-derivatives theories [6] and
even non-local theories [7] or theories in which Lorentz invariance is broken [8]. In
this Chapter we are going to discuss one possible extension of GR, the so called
Metric-Affine Gravities. These theories retain the diffeomorphism invariance of GR,
but allow the spacetime to have torsion and nonmetricity (which will be defined
below). This is achieved by allowing the affine connection used to construct co-
variant derivatives to be an independent variable and not a function of the metric
as in usual GR. The rationale of using an independent connection is that there is
no known fundamental law of physics (as far as we know) enforcing the affine con-
nection to be the Levi-Civita (LC) one usually assumed in GR. We could ask then
why in usual GR the latter is assumed. The answers are two: the first one is that
the Levi-Civita connection is the simplest possible one and when building a new
model it makes sense to start from the easiest possibility and only later increasing
the complexity, the second reason is simply that the Levi-Civita connection works in
practice. Another practical reason why MAG theories have not been very popular
in the literature is that they are very hard to handle from a computational point of
view: already GR, which is based on a two-index tensor, is much more complicated
than Yang-Mills theory, and in MAG one has to deal all the time with a three-index
tensor.

Nevertheless, in our opinion, MAG theories are a very natural extension of GR
and deserve greater attention. (In passing let us also note that thanks to the devel-
opment of computer algebra software it is today much easier to perform tensorial
computations in such theories. In particular, we want to mention the free software
packages xAct, xTensor, xPert, xTras for Mathematica, which have been used by
us for the computations of the following Chapter). From a more philosophical point
of view, another reason to study MAG theories is that their form resembles the one
of the other fundamental interactions, bringing reaserchers to investigate several
possible “gauge theories of gravity” (see [9]) for further references), with a typi-

5



cal example being given by Poincaré gauge theories (PGTs), obtained gauging the
Poincaré group. Typically, based on the analogy with Yang-Mills theory, such theo-
ries have a Lagrangian quadratic in curvature and torsion. However, in this section
we will discuss the most general Lagrangian containing terms up to dimension-four
and compatible with the symmetries. This is needed in the search for renormalizable
models (it has been shown in [10] that in general PGTs are not closed under renor-
malization, see [11, 12] for further studies of the renormalizability of MAGs) and
it is also the right context for the treatment of MAG as an Effective Field Theory
(EFT). An effective field theory is a field theory that is a good approximation of
reality below a certain energy scale Λ, above which the theory breaks down and has
to be replaced by a more fundamental one. Even though an EFT is not the ultimate
description of a system, the idea is that when the energy E of the processes under
consideration is much smaller than Λ the description given by the EFT is reliable
enough. In our particular case, we will assume that the cut-off at which possibly
the field theory description of gravity breaks down is given by the Planck mass mP

and our working hypotheses will be to consider processes well below this energy
scale. Having decided to work in a EFT framework, what we have to do now to
obtain a Lagrangian description of our system is to write all the possible operators
compatible with the assumed symmetries of the system. Of course, this would result
in an infinitely long Lagrangian that would be of no use, so what we have to do is to
order these operators according to some criterion and to limit ourselves to a subset
of them.

A standard way to classify operators in an EFT is according to the number of
derivatives of the fields. In the case of MAGs, as we shall see in the following, pro-
ceeding is such way is problematic, so we will instead order the operators according
to their canonical mass dimension. Hence, the dominant term is given by the cos-
mological constant. However, we will assume this term to be negligible, since we
are mainly interested in analysing our theories when linearized around flat space.
Now the leading terms are the dimension-two ones, then we have dimension-four
terms and so on and so forth, with terms of higher dimension becoming more and
more relevant the closer we get to the Planck scale. Focusing on the dimension-two
terms, if all the masses in the theory would be of the order of the Planck mass (this
could be considered the most natural scenario) then the only propagating particle
would in practice be the graviton and the EFT would be indistinguishable from GR.
However, even in this case, MAG is preferable to GR because it gives a dynamical
explanation for the fact that we do not observe torsion and nonmetricity in our
Universe. It could also happen that some of the massive states are lighter than
the Planck mass and so can exist as physical particle in a certain range of energies.
This could be a really interesting possibility. As we will see below, the affine con-
nection, being an object with 3 indeces, contains in principle a plethora of degrees
of freedom of several kinds (scalars, vectors, tensors) and this could give rise to a
rich and interesting phenomenology. Moreover, it could be possible to reframe some
modified theories of gravity as MAGs giving them a (maybe) stronger foundation
from a theoretical point of view. For example, a scalar-tensor theory could be seen
not as GR plus a random scalar, but as the manifestation of a propagating scalar
degree of freedom contained in the affine connection.
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This seems all good, but several things could go wrong. Considering interactions
and loop-corrections it would be difficult to explain how a possible mass hierarchy
is maintained at the full quantum level without resorting to fine tuning. A second
problem is given by the fact that the affine connection will in general contain also
a spin-3 field, whose interactions are known to be highly problematic [13]. And
even assuming to fix the problem of the spin-3 field, it is very difficult to avoid
the propagation on particles that are ghosts and tachyons [2, 14–24]. Actually the
construction of Lagrangians propagating only healthy particles is our very aim and
it will be the subject of the next Chapter. To determine which particles propagate
and their nature it is necessary to write the two-point function of the theory, also
called propagator. Since we are considering MAG as an EFT, we want to write
all the possible dimension-two and dimension-four operators compatible with diffeo-
morphism invariance and two problem arises. The first one is that the number of
such operators is huge. The second is that not all the operators are independent.
To determine the largest set of independent operator is a complicated task, but it
has been performed in [1], reference that we will follow in this Chapter to discuss
the generalities of MAG theories.

Before closing this introductory section let us observe one last thing. In ordi-
nary quantum field theory there is usually a one-to-one correspondence between the
number of fields in the Lagrangian and the number of propagating states. At the
kinematical level some Lorentz vectors and tensors carry several representation of
the three-dimensional rotation group, but only one of them is dynamical, the other
beings gauge modes. In the case of MAGs, there are known examples of ghost- and
tachyon-free theories containing more particles than fields. Again, this is due to the
fact that the affine connection is an object with 3-indeces. In the next Chapter we
will be particularly interested to what we call “simple MAGs”, namely MAG theo-
ries that behave as ordinary field theories: they propagate only a massless graviton
(either carried by the metric fluctuation or by a combination of metric fluctuation
and affine connection) and a healthy particle carried by the affine connection. The
plan of this Chapter is as follows. First, we will introduce the basic protagonists of
this and the next Chapter, and discuss the two different, although equivalent form in
which a MAG theory can be written. These are the so called Cartan form and Ein-
stein form. They describe the same physics, the former being more directly related
to geometry and the latter more directly related to particle physics and easier to use
for actual calculations. We will introduce a basic classification of MAGs depending
of the presence of torsion, curvature and nonmetricity. Next we will enumerate the
(parity-even) dimension-two and dimension-four operators relevant for the compu-
tation of the two-point function around flat spacetime. Then we will introduce the
spin-projector formalism and all the machinery required in practice to compute said
two-point function. We will close the Chapter with a concrete example of use of the
spin-projector formalism to study the spectrum of a MAG theory.

2.1 Affine connection, notations and conventions

Following [1], we use standard GR notation for the Levi-Civita connection and
standard Yang-Mills notation for the dynamically independent connection (since, as
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said above, MAG theories can be seen as a gravitational version of gauge theories)
as in the following table

coefficients covariant derivative curvature
LC connection Γµ

ρ
σ ∇µ Rµν

ρ
σ

Independent connection Aµ
ρ
σ Dµ Fµν

ρ
σ

The same symbol will be used for a given geometrical object in any frame, thus
for example Aµ

ρ
σ are the connection coefficients in a coordinate frame and Aµ

a
b are

the connection coefficients in a frame (2.1).
Since we will deal with terms involving tensors contracted in several different

ways it is useful to introduce some handy notation to make the expression more
intelligible. Given a tensor ϕabc, we define

tr(12)ϕc ≡ ϕ(12)
c = ϕa

a
c , tr(13)ϕ

b ≡ ϕ(13)b = ϕa
ba , etc.

div(1)ϕ
b
c = ∇aϕ

ab
c , div(2)ϕac = ∇bϕa

b
c , etc.

div(23)ϕc = ∇a∇bϕ
ab

c , etc.

trdiv(1)ϕ = div(1)ϕ
a
a , div tr(12)ϕ = ∇atr(12)ϕ

a , etc.

Observe that div tr(12)ϕ = trdiv(3)ϕ, etc.
We will indicate as “Div” the divergence calculate with the independent dynami-

cal connection A. In this case some care is needed when raising and lowering indices,
because the covariant derivative of the metric may not be zero. Then one has to
make conventions, for example, Div(1)ϕ

b
c = Da(g

adϕd
b
c) or Div(1)ϕ

b
c = gadDaϕd

b
c.

Let us consider an arbitrary bases {ea} in the tangent spaces and {ea} in the
cotangent spaces. In the following we will use “basis”, “frame” and “gauge” basically
as synonyms. Given a coordinate system xµ, they are related to the coordinate bases
by

ea = θa
µ∂µ , ea = θaµdx

µ . (2.1)

The transformation matrices θa
µ and θaµ are called the frame field and coframe field

(a.k.a. soldering form). The components of the metric in a general (neither natural
nor orthonormal) frame are gab and the components of a general linear connection
are Aa

b
c. The relation with the components in the coordinate bases is given by

gµν = θaµ θ
b
ν gab , (2.2)

Aλ
µ
ν = θa

µAλ
a
bθ

b
ν + θa

µ∂λθ
a
ν . (2.3)

Working with generic frames, the dynamical variables of gravity are the metric g, the
frame field θ and (in a MAG) the connection A. Moreover, the theory is invariant
under local changes of frame, i.e. local GL(4) transformations [25–30]. We can now
introduce two important geometric quantities which are typical of MAG theories,
namely the nonmetricity tensor and the torsion tensor. The nonmetricity tensor Q
is (minus) the covariant derivative of the metric and torsion is the exterior covariant
derivative of the frame field:

Qλab = −∂λgab + Aλ
c
a gcb + Aλ

c
b gac , (2.4)

Tµ
a
ν = ∂µθ

a
ν − ∂νθ

a
µ + Aµ

a
b θ

b
ν − Aν

a
b θ

b
µ . (2.5)
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Among all the possible affine connections, given a metric gab and a frame field θaµ,
there is only one for which we have both T = 0 and Q = 0. This is the so called
Levi-Civita connection. Its components are

Γabc =
1

2
(Eacb + Ecab − Ebac) −

1

2
(fabc + fcab − fbca) , (2.6)

where

Ecab = θc
λ ∂λgab , (2.7)

fbc
a =

(
θb

µ ∂µθc
λ − θc

µ ∂µθb
λ
)
θaλ . (2.8)

Note that E and f are not tensors. This expression can seem quite unfamiliar,
but this is only due to the fact that we are working in a generic basis. Let us
now consider the two most commonly used kinds of bases. The first ones are the
coordinate bases, in which

θa
µ = δµa .

The functions f vanish (since [∂µ, ∂ν ] = 0) and in the formula for the LC connection
only the first term remains. In this gauge then it is evident that Γλ

µ
ν are the familiar

Christoffel symbols. In this gauge torsion is a purely algebraic object:

Tµ
ρ
ν = Aµ

ρ
ν − Aν

ρ
µ (2.9)

whereas nonmetricity always involves a derivative of g. The second kind of bases we
want to consider are orthonormal bases. In this case the components of the metric
are given by

gab = ηab .

In this case E = 0 and in the formula for the LC connection only the second term
remains. One recognizes the resulting formula as the “spin connection”. In this
gauge the nonmetricity is a purely algebraic object:

Qcab = Acab + Acba (2.10)

whereas torsion still involves a derivative of θ.
We can now define the curvature of the independent connection, whose compo-

nents in a coordinate basis are

Fρσ
µ
ν = ∂ρAσ

µ
ν − ∂σAρ

µ
ν + Aρ

µ
λAσ

λ
ν − Aσ

µ
λAρ

λ
ν (2.11)

Following standard Yang-Mills conventions, the last two indices can be viewed as a
single index for the Lie algebra of GL(4). The same convention will be used for the
curvature of the LC connection, which is the Riemann tensor:

Rρσ
µ
ν = ∂ρΓσ

µ
ν − ∂σΓρ

µ
ν + Γρ

µ
λΓσ

λ
ν − Γσ

µ
λΓρ

λ
ν . (2.12)

An important role in determining the number of independent operators is played
by the Bianchi identities. For the independent dynamical connection, these are given
by

F[αβ
γ
δ] −D[αTβ

γ
δ] − T[α

ϵ
β|Tϵ

γ
|δ] = 0 , (2.13)

D[αFβγ]
δ
ϵ + T[α

η
β|Fη|γ]

δ
ϵ = 0 . (2.14)
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The Bianchi identities of the LC connections are the same, except that the torsion
terms are missing.

To reduce the number of fields we will work mostly in coordinate bases. This is
already a partial gauge choice since we have eliminated the freedom of choosing a
frame independently of the coordinate system and as a result some general features of
the theory could be hidden. The only remaining gauge symmetry is diffeomorphism
invariance.

2.2 The distortion

Let now be Aµ
ρ
ν a generic connection in the tangent bundle. We remind the reader

that such an object is NOT a tensor. However, the difference between two different
connections is a tensor. Given a metric gµν , we can always construct the associated
LC connection and it proves useful to decompose the connection as

Aαβγ = Γαβγ + ϕαβγ , (2.15)

where Γαβγ is the LC connection of gµν and ϕαβγ is a tensor usually called “distor-
tion” [31]. In general, the distortion has no symmetry properties. Indices are raised
and lowered with gµν . With some algebra, one finds that

Tαβγ = ϕαβγ − ϕγβα , Qαβγ = ϕαβγ + ϕαγβ . (2.16)

We can also invert these relations, to obtain the distortion as a function of torsion
and nonmetricity. We can write

ϕαβγ = Lαβγ +Kαβγ , (2.17)

where

Lαβγ =
1

2
(Qαβγ +Qγβα −Qβαγ) ,

Kαβγ =
1

2
(Tαβγ + Tβαγ − Tαγβ) . (2.18)

The tensor Kαβγ is called contortion and it is antisymmetric in the second and third
index (whereas T is antisymmetric in the first and third). The tensor Lαβγ, that
does not seem to have a commonly accepted name (it has sometime been referred to
as disformation), is symmetric in the first and third index (whereas Q is symmetric
in the second and third index). We can also write the following relations

Tαβγ = Kαβγ −Kγβα , Qαβγ = Lαβγ + Lαγβ , (2.19)

so L contains all the nonmetricity and K contains all the torsion. Another way of
saying this is that Γ + K is torsion-free and Γ + L is metric. If the reader feels
a bit confused by this proliferation of tensors we want to reassure her/him: in the
following we will express everything either in terms of ϕ or of T and Q.

Remembering that Fµν
ρ
σ is the curvature tensor of Aµ

ρ
σ, and Rµν

ρ
σ the curvature

tensor of Γµ
ρ
σ, we can relate this two objects via

Fµν
α
β = Rµν

α
β + ∇µϕ

α
ν β −∇νϕ

α
µ β + ϕ α

µ γϕ
γ

ν β − ϕ α
ν γϕ

γ
µ β . (2.20)
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In general, F is only antisymmetric in the first two indices and so it is possible to
build three independent contractions: the Ricci-like tensors

F (13)
µν = Fλµ

λ
ν , F (14)

µν = gαβFαµνβ

that do not have symmetry properties in general, and the so called homothetic
curvature

F (34)
µν = Fµν

λ
λ .

However, there is only one analog of the Ricci scalar for the connection Aµ
α
β,

namely the unique contraction Fµν
µν . Up to total derivatives, this can be written

as

Fµν
µν = R + ϕ µ

µ γϕ
γν

ν − ϕνµγϕ
µγν . (2.21)

This can be reexpressed in terms of nonmetricity and torsion as

Fµν
µν = R +

1

4
TαβγT

αβγ +
1

2
TαβγT

αγβ − tr(12)Tαtr(12)T
α

+
1

4
QαβγQ

αβγ − 1

2
QαβγQ

βαγ − 1

4
tr(23)Qαtr(23)Q

α +
1

2
tr(12)Qαtr(23)Q

α

−QαβγT
αβγ − tr(23)Qαtr(12)T

α + tr(12)Qαtr(12)T
α . (2.22)

2.3 Cartan form vs Einstein form

Any MAG can be described in two equivalent ways, depending on what connection
is used to write covariant derivatives.

• If the connection Aµ
α
β is used to write the covariant derivatives, the La-

grangian will be a combination of curvature tensors Fαβγδ, their covariant
derivatives, the tensors T , Q and their covariant derivatives DµTαβγ, DµQαβγ.
In this form, the theory is very similar to a Yang-Mills theory. This form is
called “the Cartan form” of MAG.

• If the LC connection Γµ
α
β is used to write the covariant derivatives, the La-

grangian will be a combination of the Riemann tensor Rαβγδ and its covariant
derivatives, the distortion ϕαβγ and its covariant derivatives ∇µϕαβγ, (or equiv-
alently T , Q and their covariant derivatives). In this form, MAG looks like
ordinary metric gravity coupled to a peculiar matter field. This form is called
“the Einstein form” of MAG.

Remembering the relation between the independent connection and the distor-
tion tensor, any action for a MAG in Cartan form can be rewritten in Einstein
form:

SC(g, A) = SC(g, Γ + ϕ) = SE(g, ϕ) . (2.23)

The transformation from Cartan to Einstein form is just a change of field variables.
The two forms of the theory are physically equivalent.
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It should by now be obvious that the same MAG can be written in several
different ways, depending on the choice between Cartan and Einstein form and also
depending on the choice of the frame. It is thus important to distinguish physical
statements that do not depend on the gauge (i.e. the choice of frame) or on the
choice of field variables, from statements that depend upon these choices and have
no physical content.

A great example of choice-dependent quantity is the number of derivatives of
the different terms, which in the EFT approach is often used to assess the relative
importance of different terms in the Lagrangian. In the Einstein form of MAG,
the independent fields are the metric gµν and the distortion ϕρ

µ
ν . The torsion and

nonmetricity tensors are algebraic linear combinations of the distortion and can
themselves be taken as independent dynamical variables. Thus for example, a term
like T 2 has no derivatives and counts as a mass term, while a term like (∇T )2 has
two derivatives and counts as an ordinary kinetic term. Things are different in the
Cartan form of MAG, where the nature of torsion and nonmetricity depends on the
choice of basis, i.e. on the gauge. In a general linear basis, they are the covariant
derivatives of the fundamental dynamical variables θ and g. Thus terms like T 2 or Q2

have two derivatives, while (∇T )2 or (∇Q)2 have four derivatives. Things change
if we use special frames. In coordinate frames, a term like T 2 has no derivatives
and (DT )2 has two derivatives but Q2 has two derivatives and (DQ)2 has four
derivatives. Conversely, in an orthonormal frame Q2 has no derivatives and (DQ)2

has two derivatives but T 2 has two derivatives and (DT )2 has four derivatives. It is
important to remark that the theory is always the same, despite the different way
in which it can “dress”, so the physical propagating degrees of freedom must be the
same in all these different versions of the theory. It should therefore be evident that
the derivative expansion would require great care. Here we will restrict ourselves
to the classification of the terms in the Lagrangian according to their canonical
dimension.

2.4 Basic classification of MAGs

As it should be clear from the discussion above, a general MAG theory can be quite
complicated since it involves a large number of fields. Actually the situation is
even worse since, as we will see below, the possible terms in the Lagrangian are in
the order of the hundreds already at dimension-four. To work out in detail some
concrete examples it could then be convenient to reduce in some way this complexity
and there are two main ways to achieve this: introducing kinematical constraints on
the fields or imposing additional gauge invariances, on top of diffeomorphism. Let
us briefly discuss the latter possibility. The effect of adding gauge invariances is to
make some of the components of the fields unphysical and to reduce the number of
free parameters in the Lagrangian. Gauge symmetries can be symmetries of the full
non-linear Lagrangian or symmetries of the linearized Lagrangian only. In this case
they are called “accidental symmetries”.

Let us now turn our attention to kinematical constraints. The classification of
MAGs is based on the symmetries of the distortion tensor ϕ: a MAG is symmetric
if ϕabc is symmetric in a, c, antisymmetric if ϕabc is antisymmetric in b, c, or

12



general if ϕabc has no symmetry property. 1 Then, we have the following:

• “Antisymmetric MAG”. In this case Q = 0, so the connection is metric-
compatible.

• “Symmetric MAG”. In this case T = 0, so this type of theory can be
equivalently characterized as being torsion-free.

• “General MAG”. In this case both T and Q are generally nonzero.

It is possible to impose more restrictive kinematical constraints, for example
assuming that torsion or nonmetricity are of a special form. Two possibilities con-
sidered in the literature are Tαβγ = vδϵαβγδ (this example arises in supergravity)
or Qλµν = bλgµν (as in Weyl’s theory). Another interesting case are the so-called
teleparallel theories, where one imposes Fαβγδ = 0. At the moment these are just
kinematical restrictions on the theory, without implications for the dynamics.

2.5 Lagrangians

2.5.1 Overview

In this subsection we are going to start the discussion of Lagrangians for MAG theo-
ries. We will classify the possible invariants according to their mass dimension. The
assumption is, as usual in the EFT framework, that terms of lower mass dimension
are more relevant at low energies. Let us proceed schematically for the time being,
omitting all indeces. In the Cartan form of the theory the covariant field strengths
are the curvature F , of mass dimension two, and the torsion T and nonmetricity
Q, both of mass dimension one. Thus the possible dimension-two terms in the La-
grangian are either linear in F or quadratic in T and Q and their coefficients will
have dimension of mass squared. Moving to dimension-four terms, these are of the
forms F 2, F DT , F DQ, cubic in T and Q with one derivative or quartic in T
and Q. These terms have dimensionless coefficients. Let us call a the coeffcients of
dimension-two terms and c the coeffients of dimension-fours terms. A superscript
will indicate the type of term they multiply. When indices will be reintroduced, the
different couplings will be identified also using a subscript number. The schematic
form of the Lagrangian is the following

LC = aFF + aTTTT + aTQTQ+ aQQQQ

+cFFFF + cFTFDT + cFQFDQ+ cTT (DT )2 + cTQDTDQ+ cQQ(DQ)2

+cFTTFTT + cFTQFTQ+ cFQQFQQ

+cTTTTTDT + . . .+ cQQQQQDQ

+cTTTTTTTT + . . .+ cQQQQQQQQ , (2.24)

1A three-index tensor that is simultaneously symmetric in one pair of indices and antisymmetric
in another is zero. Thus a MAG that is simultaneously symmetric and antisymmetric is not a MAG
- it does not have an independent connection.
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The action in Einstein form is obtained using ∇ = D + ϕ and expressing T , Q
and F in terms of ϕ. Schematically

F ∼ R + ∇ϕ+ ϕϕ , T ∼ ϕ , Q ∼ ϕ .

Then the Lagrangian in Einstein form is

LE = mRR +mϕϕϕϕ

+bRRRR + bRϕR∇ϕ+ bϕϕ(∇ϕ)2

+bRϕϕRϕϕ+ bϕϕϕϕϕ∇ϕ+ bϕϕϕϕϕϕϕϕ , (2.25)

where the dimension-two couplings are now called m and the dimensionless ones
are called b. This is the most general Lagrangian for the Einstein form of MAG,
involving terms of dimension two and four. This Lagrangian can be recast in a
different form expressing ϕ in terms of T and Q. Note however that in this case
T and Q have to be considered as independent variables, while in the Lagrangian
written in Cartan form they are understood as functions of A and g. To avoid
confusion, in LE the coefficients will be called bRT , bRQ, bTT etc. In the following
we will be mainly interested in the linearization of the theory around flat space, so
the terms we should care for are the ones quadratic in the fields, the others can be
considered interaction terms. As a final remark, while the dependence on the metric
is non-polynomial, the dependence on distortion is at most quartic.

2.5.2 Dimension-two terms

Let us start our analysis looking at dimension-two terms. In Cartan form, the
Lagrangian is

L(2)
C = −1

2

[
−aFF +

3∑
i=1

aTT
i MTT

i +
3∑

i=1

aTQ
i MTQ

i +
5∑

i=1

aQQ
i MQQ

i

]
, (2.26)

where F = Fµν
µν is the unique scalar that can be constructed from the curvature

and aF = m2
P , where mP is the Planck mass. This will be called Palatini term. The

other scalars are

MTT
1 = T µρνTµρν , MTT

2 = T µρνTµνρ , MTT
3 = tr(12)T

µtr(12)Tµ ,

MQQ
1 = QρµνQρµν , MQQ

2 = QρµνQνµρ ,

MQQ
3 = tr(23)Q

µtr(23)Qµ , MQQ
4 = tr(12)Q

µtr(12)Qµ , MQQ
5 = tr(23)Q

µtr(12)Qµ ,

MTQ
1 = T µρνQµρν , MTQ

2 = tr(12)T
µtr(23)Qµ , MTQ

3 = tr(12)T
µtr(12)Qµ . (2.27)

We can recast the Lagrangian in Einstein form obtaining

L(2)
E = −1

2

[
−mRR +

11∑
i=1

mϕϕ
i Mϕϕ

i

]
, (2.28)

where

Mϕϕ
1 = ϕµνρϕ

µνρ , Mϕϕ
2 = ϕµνρϕ

µρν , Mϕϕ
3 = ϕµνρϕ

ρνµ , Mϕϕ
4 = ϕµνρϕ

νµρ , Mϕϕ
5 = ϕµνρϕ

νρµ ,

Mϕϕ
6 = tr(12)ϕµtr(12)ϕ

µ , Mϕϕ
7 = tr(13)ϕµtr(13)ϕ

µ , Mϕϕ
8 = tr(23)ϕµtr(23)ϕ

µ ,

Mϕϕ
9 = tr(12)ϕµtr(13)ϕ

µ , Mϕϕ
10 = tr(12)ϕµtr(23)ϕ

µ , Mϕϕ
11 = tr(13)ϕµtr(23)ϕ

µ . (2.29)
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The first term is now the usual Einstein-Hilbert Lagrangian and the rest are mass
terms for ϕ. The correspondence between the parameters mi and ai is

mR = aF , mϕϕ
1 = 2aTT

1 + 2aQQ
1 + aTQ

1 , mϕϕ
2 = aTT

2 + 2aQQ
1 + aTQ

1 ,

mϕϕ
3 = −2aTT

1 + aQQ
2 − aTQ

1 , mϕϕ
4 = aTT

2 + aQQ
2 , mϕϕ

5 = aF − 2aTT
2 + 2aQQ

2 − aTQ
1 ,

mϕϕ
6 = aTT

3 + aQQ
4 + aTQ

3 , mϕϕ
7 = aQQ

4 , mϕϕ
8 = aTT

3 + 4aQQ
3 − 2aTQ

2 ,

mϕϕ
9 = −aF + 2aQQ

4 + aTQ
3 , mϕϕ

10 = −2aTT
3 + 2aQQ

5 + 2aTQ
2 − aTQ

3 , mϕϕ
11 = 2aQQ

5 − aTQ
3 .

(2.30)

Expressing ϕ in terms of T and Q we obtain

L(2)
E = −1

2

[
−mRR +

3∑
i=1

mTT
i MTT

i +
3∑

i=1

mTQ
i MTQ

i +
5∑

i=1

mQQ
i MQQ

i

]
, (2.31)

where T , Q are now independent variables and

mTT
1 = aTT

1 − 1

4
aF , mTT

2 = aTT
2 − 1

2
aF , mTT

3 = aTT
3 + aF ,

mQQ
1 = aQQ

1 − 1

4
aF , mQQ

2 = aQQ
2 +

1

2
aF , mQQ

3 = aQQ
3 +

1

4
aF ,

mQQ
4 = aQQ

4 , mQQ
5 = aQQ

5 − 1

2
aF ,

mTQ
1 = aTQ

1 + aF , mTQ
2 = aTQ

2 + aF , mTQ
3 = aTQ

3 − aF . (2.32)

These formulae can be specialized to antisymmetric and symmetric MAG, simply
setting Q = 0 and T = 0, respectively.

2.5.3 Dimension-four terms in Einstein form

The counting of independent terms is easier in the Einstein point of view, where the
variables are (g, ϕ). In the following, scalar monomials in the fields which appear in
the Lagrangian will be called “invariants”. In the Einstein form of the theory, they
will be denoted

HX,Y
i where X, Y ∈ {R, T,Q}

and i is an index labelling different monomials. We will present at first the results
for antisymmetric MAG, which is simplest, then for symmetric MAG and finally for
the general case.

Antisymmetric MAG á la Einstein

Let us start from the subclass of antisymmetric MAGs, taking g and T as basic
variables. The numbers of independent terms or each type is

R2 (∇T )2 R∇T RT 2 T 2∇T T 4 Total
3 9 2 14 31 33 92
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Since our aim it to compute the two-point functions around flat space, only the
terms in the first three columns are relevant for us. Let see more closely what they
look like. There are three RR terms

HRR
1 = RµνρσR

µνρσ , HRR
2 = RµνR

µν , HRR
3 = R2 , (2.33)

nine (∇T )2 terms

HTT
1 = ∇αT βγδ∇αTβγδ , HTT

2 = ∇αT βγδ∇αTβδγ ,
HTT

3 = ∇αtr(12)T
β∇αtr(12)Tβ ,

HTT
4 = div(1)T

αβdiv(1)Tαβ , HTT
5 = div(1)T

αβdiv(1)Tβα ,
HTT

6 = div(2)T
αβdiv(2)Tαβ , HTT

7 = div(1)T
αβdiv(2)Tαβ ,

HTT
8 = div(2)T

αβ∇αtr(12)Tβ , HTT
9 = (trdiv(1)T )2 ,

(2.34)

and considering the independent contractions one has five R∇T -type terms

HRT
1 = Rαβγδ∇αTβγδ , HRT

2 = Rαγβδ∇αTβγδ ,
HRT

3 = Rβγdiv(1)Tβγ , HRT
4 = Rαβ∇αtr(12)Tβ , HRT

5 = R trdiv(1)T .

(2.35)

However, these invariants are not all independent. In fact contracting the first
(algebraic) Bianchi identity with ∇T one obtains the relation

HRT
2 = 2HRT

1 , (2.36)

while using the second Bianchi identity, contracted with T , and integrating by parts
the following relations are obtained:

HRT
3 = HRT

1 ,

HRT
5 = −2HRT

4 . (2.37)

The authors of [?] chose to of keep

{HRT
3 , HRT

5 } (2.38)

as independent invariants of type R∇T . Thus, there are 3 + 9 + 2 = 14 independent
terms quadratic in the fields.

In the table the number of interaction terms is also given. This was computed
in [1] using the function AllContractions of the xTras package for Mathematica.
We report their findings. For the RTT terms, there are 18 different contractions,
but the first Bianchi identity, contracted with TT , gives 4 relations between these
terms, leading to 14. For TT∇T , AllContractions gives 46 terms, but there are
15 total derivative terms of this type, so the number of independent ones is 31. 2

2The number of total derivative terms can be determined applying AllContractions to qTTT ,
where qµ is any vector (it can be thought of as the momentum).
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Symmetric MAG á la Einstein

For symmetric (torsionfree) theories, one can use g and Q as fundamental variables.
Then, the counting of dimension-four terms gives:

R2 (∇Q)2 R∇Q RQ2 Q2∇Q Q4 Total
3 16 4 22 59 69 173

The quadratic invariants are the three R2 terms already listed above, plus the fol-
lowing (∇Q)2 terms

HQQ
1 = ∇αQβγδ ∇αQβγδ , HQQ

2 = ∇αQβγδ ∇αQγβδ ,

HQQ
3 = ∇αtr(12)Q

β ∇αtr(12)Qβ , HQQ
4 = ∇αtr(23)Q

β ∇αtr(23)Qβ ,

HQQ
5 = ∇αtr(12)Q

β ∇αtr(23)Qβ ,

HQQ
6 = div(1)Q

αβ div(1)Qαβ , HQQ
7 = div(2)Q

αβ div(2)Qαβ ,

HQQ
8 = div(2)Q

αβ div(2)Qβα , HQQ
9 = div(1)Q

αβ div(2)Qαβ ,

HQQ
10 = div(2)Q

αβ∇αtr(12)Qβ , HQQ
11 = div(2)Q

αβ∇αtr(23)Qβ ,

HQQ
12 = div(2)Q

αβ∇βtr(12)Qα , HQQ
13 = div(2)Q

αβ∇βtr(23)Qα ,

HQQ
14 = (trdiv(1)Q)2 , HQQ

15 = (trdiv(2)Q)2 ,

HQQ
16 = trdiv(1)Q trdiv(2)Q ,

(2.39)

and the R∇Q terms

HRQ
1 = Rαγβδ∇αQβγδ , HRQ

2 = Rαβ∇αtr(12)Qβ , HRQ
3 = Rαβ∇βtr(23)Qα ,

HRQ
4 = Rαβ div(1)Qαβ , HRQ

5 = Rαβ div(2)Qαβ ,

HRQ
6 = R trdiv(1)Q , HRQ

7 = R trdiv(2)Q .

(2.40)

Also in this case, not all these invariants are independent. Using the second
Bianchi identity contracted with Q, and allowing integrations by parts, one obtains
the three relations

HRQ
1 = HRQ

4 −HRQ
5 ,

2HRQ
2 = HRQ

7 ,

2HRQ
3 = HRQ

6 . (2.41)

For example, one can solve for HRQ
1 , HRQ

2 , HRQ
3 and keep

{HRQ
4 , HRQ

5 , HRQ
6 , HRQ

7 } (2.42)

as independent invariants. There are therefore 3+16+4 = 23 independent invariants
quadratic in the fields.

The numbers of cubic and quartic interaction terms can be determined as in
the previous subsection. AllContractions gives 23 terms of the type RQQ, and
the first Bianchi identity contracted with QQ gives one relation between them,
bringing the number of independent terms of this type to 22. For QQ∇Q terms,
AllContractions gives 95 terms, but 36 of them are total derivatives, so the number
of independent ones is 59.
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General MAG á la Einstein

In the general case the counting is simpler if one uses ϕ as a variable, rather than
T and Q. Then one has

R2 (∇ϕ)2 R∇ϕ Rϕ2 ϕ2∇ϕ ϕ4 Total
3 38 6 56 315 504 922

The list of the (∇ϕ)2 terms is 3

Hϕϕ
1 = ∇αϕβγδ∇αϕβγδ , Hϕϕ

2 = ∇αϕβγδ∇αϕβδγ , Hϕϕ
3 = ∇αϕβγδ∇αϕδγβ ,

Hϕϕ
4 = ∇αϕβγδ∇αϕγβδ , Hϕϕ

5 = ∇αϕβγδ∇αϕδβγ ,

Hϕϕ
6 = ∇αtr(12)ϕ

β∇αtr(12)ϕβ , Hϕϕ
7 = ∇αtr(13)ϕ

β∇αtr(13)ϕβ , Hϕϕ
8 = ∇αtr(23)ϕ

β∇αtr(23)ϕβ ,

Hϕϕ
9 = ∇αtr(12)ϕ

β∇αtr(13)ϕβ , Hϕϕ
10 = ∇αtr(12)ϕ

β∇αtr(23)ϕβ , Hϕϕ
11 = ∇αtr(13)ϕ

β∇αtr(23)ϕβ ,

Hϕϕ
12 = div(1)ϕ

αβdiv(1)ϕαβ , Hϕϕ
13 = div(1)ϕ

αβdiv(1)ϕβα ,

Hϕϕ
14 = div(2)ϕ

αβdiv(2)ϕαβ , Hϕϕ
15 = div(2)ϕ

αβdiv(2)ϕβα ,

Hϕϕ
16 = div(3)ϕ

αβdiv(3)ϕαβ , Hϕϕ
17 = div(3)ϕ

αβdiv(3)ϕβα ,

Hϕϕ
18 = div(1)ϕ

αβdiv(2)ϕαβ , Hϕϕ
19 = div(1)ϕ

αβdiv(2)ϕβα ,

Hϕϕ
20 = div(1)ϕ

αβdiv(3)ϕαβ , Hϕϕ
21 = div(1)ϕ

αβdiv(3)ϕβα ,

Hϕϕ
22 = div(2)ϕ

αβdiv(3)ϕαβ , Hϕϕ
23 = div(2)ϕ

αβdiv(3)ϕβα ,

Hϕϕ
24 = div(1)ϕ

αβ∇αtr(12)ϕβ , Hϕϕ
25 = div(1)ϕ

αβ∇αtr(13)ϕβ , Hϕϕ
26 = div(1)ϕ

αβ∇αtr(23)ϕβ ,

Hϕϕ
27 = div(3)ϕ

αβ∇αtr(12)ϕβ , Hϕϕ
28 = div(3)ϕ

αβ∇αtr(13)ϕβ , Hϕϕ
29 = div(3)ϕ

αβ∇αtr(23)ϕβ ,

Hϕϕ
30 = div(2)ϕ

αβ∇βtr(12)ϕα , Hϕϕ
31 = div(2)ϕ

αβ∇βtr(13)ϕα , Hϕϕ
32 = div(2)ϕ

αβ∇βtr(23)ϕα ,

Hϕϕ
33 = (trdiv(1)ϕ)2 , Hϕϕ

34 = (trdiv(2)ϕ)2 , Hϕϕ
35 = (trdiv(3)ϕ)2 ,

Hϕϕ
36 = trdiv(1)ϕ trdiv(2)ϕ , Hϕϕ

37 = trdiv(1)ϕ trdiv(3)ϕ , Hϕϕ
38 = trdiv(2)ϕ trdiv(3)ϕ .

(2.43)

Note that the contraction of indices in the terms Hϕϕ
30 - Hϕϕ

32 is different from the
order in the preceding six terms. This is necessary to make them independent. In
fact those nine terms can be rewritten as

Hϕϕ
24 = −div(12)ϕ

αtr(12)ϕα , Hϕϕ
25 = −div(12)ϕ

αtr(13)ϕα , Hϕϕ
26 = −div(12)ϕ

αtr(23)ϕα ,

Hϕϕ
27 = −div(13)ϕ

αtr(12)ϕα , Hϕϕ
28 = −div(13)ϕ

αtr(13)ϕα , Hϕϕ
29 = −div(13)ϕ

αtr(23)ϕα ,

Hϕϕ
30 = −div(23)ϕ

αtr(12)ϕα , Hϕϕ
31 = −div(23)ϕ

αtr(13)ϕα , Hϕϕ
32 = −div(23)ϕ

αtr(23)ϕα .

(2.44)

The R∇ϕ terms are

HRϕ
1 = Rαβγδ∇αϕβγδ , HRϕ

2 = Rαβγδ∇δϕαγβ , HRϕ
3 = Rαβγδ∇δϕαβγ ,

HRϕ
4 = Rαβ∇αtr(12)ϕβ , HRϕ

5 = Rαβ∇αtr(13)ϕβ , HRϕ
6 = Rαβ∇αtr(23)ϕβ ,

HRϕ
7 = Rαβdiv(1)ϕαβ , HRϕ

8 = Rαβdiv(2)ϕαβ , HRϕ
9 = Rαβdiv(3)ϕαβ ,

HRϕ
10 = R trdiv(1)ϕ , HRϕ

11 = R trdiv(2)ϕ , HRϕ
12 = R trdiv(3)ϕ .

(2.45)

3Note that up to terms of the form R∇ϕ, div(1)ϕ
αβ∇βtr(12)ϕα = div(3)ϕ

αβ∇αtr(12)ϕβ etc.
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Again, it is possible to reduce the number of independent invariants using Bianchi
identities. The first Bianchi identity for ∇ contracted with ∇ϕ gives the relation

HRϕ
1 +HRϕ

2 −HRϕ
3 = 0 , (2.46)

Contracting the second Bianchi identity with ϕ and using integrations by parts, one
finds:

HRϕ
1 −HRϕ

8 +HRϕ
9 = 0 ,

HRϕ
2 +HRϕ

7 −HRϕ
9 = 0 ,

HRϕ
3 +HRϕ

7 −HRϕ
8 = 0 ,

2HRϕ
4 −HRϕ

12 = 0 ,

2HRϕ
5 −HRϕ

11 = 0 ,

2HRϕ
6 −HRϕ

10 = 0 . (2.47)

A linear combination of the first three is equivalent to (2.46), so there are six inde-
pendent relations. Using these it is possible to eliminate six invariants, bringing the
number of R∇ϕ terms from 12 to 6, as indicated in the table. For example, one can
solve for HRϕ

1 , HRϕ
2 , HRϕ

3 , HRϕ
4 , HRϕ

5 , HRϕ
6 and keep

{HRϕ
7 , HRϕ

8 , HRϕ
9 , HRϕ

10 , HRϕ
11 , HRϕ

12 } (2.48)

as independent invariants. There are therefore 3+38+6 = 47 independent invariants
quadratic in the fields.

In the following we will mostly use T and Q as independent fields instead of ϕ.
Then the kinetic terms for these fields would be given by the invariants listed in the
previous subsections and by the following ∇T∇Q terms:

HTQ
1 = ∇αT βγδ ∇αQβγδ , HTQ

2 = ∇αtr(12)T
β ∇αtr(12)Qβ ,

HTQ
3 = ∇αtr(12)T

β ∇αtr(23)Qβ ,

HTQ
4 = div(1)T

αβ div(1)Qαβ , HTQ
5 = div(2)T

αβ div(2)Qαβ ,

HTQ
6 = div(1)T

αβ div(2)Qαβ , HTQ
7 = div(1)T

αβ div(2)Qβα ,

HTQ
8 = div(2)T

αβ∇αtr(12)Qβ , HTQ
9 = div(2)T

αβ∇αtr(23)Qβ ,

HTQ
10 = div(2)Q

αβ∇αtr(12)Tβ , HTQ
11 = div(2)Q

αβ∇βtr(12)Tα ,

HTQ
12 = trdiv(1)T trdiv(1)Q , HTQ

13 = trdiv(1)T trdiv(2)Q .

(2.49)

There are 9 (∇T )2 terms, 16 (∇Q)2 terms and 13 ∇T∇Q terms for a total of 38
terms, that can be used interchangeably with the 38 (∇ϕ)2 terms listed above. A
basis for the quadratic terms is given by these 38 terms, plus the three R2 terms,
plus

{HRT
3 , HRT

5 , HRQ
4 , HRQ

5 , HRQ
6 , HRQ

7 } , (2.50)

for a total of 47 terms.
For the cubic interactions, AllContractions gives 65 terms of the type Rϕϕ,

but the first Bianchi identity, contracted with ϕϕ, gives 9 relations between them,
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so that the number of independent ones is 56. 4 AllContractions also gives 483
terms of the form ϕϕ∇ϕ, out of which 168 are total derivatives, so the number of
independent ones is 315. The numbers are obviously the same if one uses T and Q
as variables.

2.5.4 Dimension-four terms in Cartan form

The counting of the possible terms in the Lagrangian in the Cartan form of the
theory is more difficult. The invariants that can appear in the Lagrangian in Cartan
form are denoted

LX,Y
i , where X, Y ∈ {F, T,Q} ,

to distinguish them from the HXY
i of the Einstein form of the theory. We will begin

by listing all the possible terms.
FF terms:

LFF
1 = F µνρσFµνρσ , LFF

2 = F µνρσFµνσρ , LFF
3 = F µνρσFρσµν ,

LFF
4 = F µνρσFµρνσ , LFF

5 = F µνρσFµσνρ , LFF
6 = F µνρσFµσρν ,

LFF
7 = F (13)µνF (13)

µν , LFF
8 = F (13)µνF (13)

νµ ,

LFF
9 = F (14)µνF (14)

µν , LFF
10 = F (14)µνF (14)

νµ ,

LFF
11 = F (13)µνF (14)

µν , LFF
12 = F (13)µνF (14)

νµ ,

LFF
13 = F (34)µνF (34)

µν , LFF
14 = F (34)µνF (13)

µν , LFF
15 = F (34)µνF (14)

µν ,

LFF
16 = F 2 . (2.51)

(DT )2 terms:

LTT
1 = DαT βγδDαTβγδ , LTT

2 = DαT βγδDαTβδγ ,
LTT
3 = Dαtr(12)T

βDαtr(12)Tβ ,
LTT
4 = Div(1)T

αβDiv(1)Tαβ , LTT
5 = Div(1)T

αβDiv(1)Tβα ,
LTT
6 = Div(2)T

αβDiv(2)Tαβ , LTT
7 = Div(1)T

αβDiv(2)Tαβ ,
LTT
8 = Div(2)T

αβDαtr(12)Tβ , LTT
9 = (trDiv(1)T )2 .

(2.52)

(DQ)2 terms:

LQQ
1 = DαQβγδDαQβγδ , LQQ

2 = DαQβγδDαQγβδ ,

LQQ
3 = Dαtr(12)Q

β Dαtr(12)Qβ , LQQ
4 = Dαtr(23)Q

β Dαtr(23)Qβ ,

LQQ
5 = Dαtr(12)Q

β Dαtr(23)Qβ ,

LQQ
6 = Div(1)Q

αβ Div(1)Qαβ , LQQ
7 = Div(2)Q

αβ Div(2)Qαβ ,

LQQ
8 = Div(2)Q

αβ Div(2)Qβα , LQQ
9 = Div(1)Q

αβ Div(2)Qαβ ,

LQQ
10 = Div(2)Q

αβ Dαtr(12)Qβ , LQQ
11 = Div(2)Q

αβ Dαtr(23)Qβ ,

LQQ
12 = Div(2)Q

αβ Dβtr(12)Qα , LQQ
13 = Div(3)Q

αβ Dβtr(23)Qα ,

LQQ
14 = (trDiv(1)Q)2 , LQQ

15 = (trDiv(2)Q)2 ,

LQQ
16 = trDiv(1)Q trDiv(2)Q .

(2.53)

4The nine relations can be most easily counted in terms of Rϕϕ, but they are equivalent to the
4 relations already mentioned for the RTT terms, one relation already mentioned for the RQQ
terms and four additional ones for the RTQ terms.
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DTDQ terms

LTQ
1 = DαT βγδDαQβγδ , LTQ

2 = Dαtr(12)T
β Dαtr(12)Qβ ,

LTQ
3 = Dαtr(12)T

β Dαtr(23)Qβ ,

LTQ
4 = Div(1)T

αβ Div(1)Qαβ , LTQ
5 = Div(2)T

αβ Div(2)Qαβ ,

LTQ
6 = Div(1)T

αβ Div(2)Qαβ , LTQ
7 = Div(1)T

αβ Div(2)Qβα ,

LTQ
8 = Div(2)T

αβDαtr(12)Qβ , LTQ
9 = Div(2)T

αβDαtr(23)Qβ ,

LTQ
10 = Div(2)Q

αβDαtr(12)Tβ , LTQ
11 = Div(2)Q

αβDβtr(12)Tα ,

LTQ
12 = trDiv(1)T trDiv(1)Q , LTQ

13 = trDiv(1)T trDiv(2)Q .

(2.54)

FDT terms:

LFT
1 = F µνρσDµTνρσ , LFT

2 = F µνρσDµTνσρ , LFT
3 = F µνρσDµTρνσ ,

LFT
4 = F µνρσDρTµνσ , LFT

5 = F µνρσDρTµσν , LFT
6 = F µνρσDσTµνρ ,

LFT
7 = F µνρσDσTµρν ,

LFT
8 = F (13)µνDµtr(12)Tν , LFT

9 = F (13)µνDνtr(12)Tµ ,
LFT
10 = F (14)µνDµtr(12)Tν , LFT

11 = F (14)µνDνtr(12)Tµ , LFT
12 = F (34)µνDµtr(12)Tν ,

LFT
13 = F (13)µν Div(1)Tµν , LFT

14 = F (13)µν Div(1)Tνµ ,
LFT
15 = F (14)µν Div(1)Tµν , LFT

16 = F (14)µν Div(1)Tνµ ,
LFT
17 = F (13)µν Div(2)Tµν , LFT

18 = F (14)µν Div(2)Tµν ,
LFT
19 = F (34)µν Div(1)Tµν , LFT

20 = F (34)µν Div(2)Tµν , LFT
21 = F trDiv(1)T .

(2.55)

FDQ terms:

LFQ
1 = F µνρσDµQνρσ , LFQ

2 = F µνρσDνQρσµ , LFQ
3 = F µνρσDνQσρµ ,

LFQ
4 = F µνρσDρQµνσ , LFQ

5 = F µνρσDσQµνρ ,

LFQ
6 = F (13)µνDµtr(12)Qν , LFQ

7 = F (13)µνDνtr(12)Qµ ,

LFQ
8 = F (13)µνDµtr(23)Qν , LFQ

9 = F (13)µνDνtr(23)Qµ ,

LFQ
10 = F (14)µνDµtr(12)Qν , LFQ

11 = F (14)µνDνtr(12)Qµ ,

LFQ
12 = F (14)µνDµtr(23)Qν , LFQ

13 = F (14)µνDνtr(23)Qµ ,

LFQ
14 = F (34)µνDµtr(12)Qν , LFQ

15 = F (34)µνDµtr(23)Qν ,

LFQ
16 = F (13)µν Div(1)Qµν , LFQ

17 = F (14)µν Div(1)Qµν ,

LFQ
18 = F (13)µν Div(2)Qµν , LFQ

19 = F (13)µν Div(2)Qνµ ,

LFQ
20 = F (14)µν Div(2)Qµν , LFQ

21 = F (14)µν Div(2)Qνµ , LFQ
22 = F (34)µν Div(2)Qµν ,

LFQ
23 = F trDiv(1)Q , LFQ

24 = F trDiv(2)Q .

(2.56)

It is worth noting that whereas the 38 terms LTT , LQQ, LTQ in (2.52,2.53,2.54) are in
one-to-one correspondence with the terms HTT , HQQ, HTQ in (2.34,2.39,2.49), there
are many more terms of type FF , FDT , FDQ than RR, R∇T , R∇Q. This is due
to the fact that the curvature tensor F has less symmetries than the Riemann tensor.
This also means that there will also be many more relations. We will now gradually
discover these relations and we will build a basis of invariants. The counting of cubic
and quartic interaction terms would be overly complicated. However ultimately they
will be in one-to-one correspondence with those of the Einstein formulation, that
have been counted in the previous sections.
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Antisymmetric MAG á la Cartan

Let us start listing all the quadratic invariants. In antisymmetric MAG F is anti-
symmetric in both pairs of indices, hence there are fewer independent terms than in
general MAG. The choice done in [1] is to retain LFF

i with i = 1, 3, 4, 7, 8, 16, while

LFF
2 = −LFF

1 , LFF
5 = −LFF

4 , LFF
6 = LFF

4 ,

LFF
9 = LFF

7 , LFF
10 = LFF

8 , LFF
11 = −LFF

7 , LFF
12 = −LFF

8 ,

LFF
13 = LFF

14 = LFF
15 = 0 . (2.57)

All the terms LTT are kept. They are the same as the invariants of type (∇T )2, ex-
cept for the replacement of ∇ byD. We keep also LFT

i with i = 1, 3, 4, 5, 8, 9, 13, 14, 17, 21,
while

LFT
2 = −LFT

1 , LFT
6 = −LFT

4 , LFT
7 = −LFT

5 ,

LFT
10 = −LFT

8 , LFT
11 = −LFT

9 , LFT
15 = −LFT

13 , LFT
16 = −LFT

14 ,

LFT
18 = −LFT

17 , LFT
12 = LFT

19 = LFT
20 = 0 . (2.58)

So far there are 25 quadratic terms, compared to the 14 quadratic terms in the
Einstein form of antisymmetric MAG. However, as anticipated, now there are several
additional relations. Multiplying (2.13) by F , one obtains, up to interaction term
of the form FTT ,

LFT
8 − LFT

9 − LFT
17 = −LFF

7 + LFF
8 ,

−2LFT
1 + LFT

5 = −LFF
1 + 2LFF

4 ,

LFT
3 − 2LFT

4 = −LFF
3 + 2LFF

4 , (2.59)

and multiplying (2.14) by T (and using integrations by parts) gives, again up to
terms of the form FTT ,

LFT
5 − 2LFT

14 = 0 ,

−LFT
4 + LFT

13 − LFT
17 = 0 ,

2LFT
9 + LFT

21 = 0 . (2.60)

Furthermore, multiplying (2.13) by ∇T gives, up to terms cubic in T ,

LFT
17 = 1/2LTT

6 − LTT
8 ,

LFT
13 − LFT

14 = LTT
7 − LTT

8 ,

LFT
8 − LFT

9 = −LTT
3 + LTT

8 + LTT
9 ,

2LFT
4 − LFT

5 = −LTT
6 + 2LTT

7 ,

LFT
1 − LFT

3 + LFT
4 = −LTT

2 + LTT
5 + LTT

7 ,

2LFT
1 − LFT

5 = LTT
1 − 2LTT

4 . (2.61)

In total it is possible to obtain 12 relations, of which 11 are linearly independent.
Hence it is possible to eliminate 22 out the 36 invariants listed in (2.51,2.52,2.55),
and we remain with 14 independent quadratic invariants, exactly as in the counting
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in the Einstein form. There are different possible ways of solving these relations, let
see two of them. The first is to retain all the nine LTT terms, plus

{LFF
1 , LFF

7 , LFF
16 } and {LFT

13 , LFT
21 } , (2.62)

which is in one-to-one correspondence with (2.33) and (2.38). Thus, the elements
of this basis are in one-to-one correspondence with the elements of the basis in
the Einstein form, from which they are obtained just by replacing R → F and
∇ → D. Since the curvature has a geometrical meaning, when we use the inde-
pendent connection A, it might be desirable to keep all terms that contain F , and
instead remove others. A possible basis is obtained using the six LFF invariants
{LFF

1 , LFF
3 , LFF

4 , LFF
7 , LFF

8 , LFF
16 }, plus

{LTT
1 , LTT

2 , LTT
3 , LTT

5 } and {LFT
1 , LFT

8 , LFT
9 , LFT

13 } . (2.63)

Symmetric MAG á la Cartan

In symmetric (torsionfree) MAG, the curvature tensor is only antisymmetric in the
first pair of indices, but the first Bianchi identity (2.13) leads to six independent
relations

LFF
1 − 2LFF

6 = 0 ,

LFF
2 − 2LFF

5 = 0 ,

LFF
3 − LFF

4 + LFF
5 = 0 ,

LFF
13 + 2LFF

14 = 0 ,

LFF
7 − LFF

8 + LFF
14 = 0 ,

LFF
11 − LFF

12 + LFF
15 = 0 . (2.64)

This reduces the number of independent curvature squared terms to 10. Keeping
the invariants LFF

i with i = 1, 2, 3, 7, 8, 9, 10, 11, 12, 16 and solving for the others:

LFF
4 = 1/2LFF

2 + LFF
3 , LFF

5 = 1/2LFF
2 ,

LFF
6 = 1/2LFF

1 , LFF
13 = 2(LFF

7 − LFF
8 ) ,

LFF
14 = −LFF

7 + LFF
8 , LFF

15 = −LFF
11 + LFF

12 . (2.65)

Multiplying (2.13) by DQ one obtains, up to interaction terms, the relations

LFQ
18 − LFQ

19 + LFQ
22 = 0 ,

LFQ
6 − LFQ

7 + LFQ
14 = 0 ,

LFQ
8 − LFQ

9 + LFQ
15 = 0 ,

LFQ
1 + LFQ

3 + LFQ
5 = 0 , (2.66)

and multiplying (2.14) by Q one obtains, again up to interaction terms, the relations

LFQ
7 − LFQ

11 − LFQ
24 = 0 ,

LFQ
9 − LFQ

13 − LFQ
23 = 0 ,

LFQ
5 − LFQ

17 + LFQ
20 = 0 ,

LFQ
4 − LFQ

16 + LFQ
18 = 0 . (2.67)
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In this case the Bianchi identities are not enough to uncover all the relations and
another method is needed. It is possible to use (2.20) in the FF terms; this will
give among other things RR terms, R∇T and R∇Q. Then one looks for linear
combinations of the FF terms such that these terms involving R in the r.h.s. cancel
out. In this way, up to cubic and quartic terms, it is possible to relate FF terms to
(DT )2 terms etc. From the FF terms one obtains

LFF
1 + LFF

2 = LQQ
1 − LQQ

6 ,

2(LFF
1 − LFF

3 ) = 3LQQ
1 − 2LQQ

2 − 3LQQ
6 − 2LQQ

7 + 4LQQ
9 ,

4(LFF
7 − LFF

8 ) = LQQ
4 − LQQ

14 ,

4(LFF
9 − LFF

10 ) = 4LQQ
3 + LQQ

4 − 4LQQ
5 + 4LQQ

7 − 4LQQ
8 − 8LQQ

10

+4LQQ
11 + 8LQQ

12 − 4LQQ
13 − LQQ

14 − 4LQQ
15 + 4LQQ

16 ,

4(LFF
11 − LFF

12 ) = −LQQ
4 + 2LQQ

5 − 2LQQ
11 + 2LQQ

13 + LQQ
14 − 2LQQ

16 ,

LFF
7 +LFF

8 +LFF
9 +

LFF
10 +2LFF

11 +2LFF
12 = LQQ

3 +LQQ
7 +LQQ

8 −2LQQ
10 −2LQQ

12 +LQQ
15 . (2.68)

Operating in a similar way on the FDQ terms one obtains

2LFQ
1 = LQQ

1 − LQQ
6 ,

LFQ
2 + LFQ

3 = −LQQ
2 + LQQ

9 ,

2(LFQ
2 + LFQ

4 ) = LQQ
1 − 2LQQ

2 − LQQ
6 − 2LQQ

7 + 4LQQ
9 ,

2(LFQ
2 − LFQ

5 ) = LQQ
1 − 2LQQ

2 − LQQ
6 + 2LQQ

9 ,

2(LFQ
6 − LFQ

7 ) = −LQQ
5 + LQQ

16 ,

LFQ
6 + LFQ

10 = −LQQ
3 + LQQ

10 ,

2(LFQ
10 − LFQ

11 ) = −2LQQ
3 + LQQ

5 + 2LQQ
10 − 2LQQ

12 + 2LQQ
15 − LQQ

16 ,

2(LFQ
8 − LFQ

9 ) = −LQQ
4 + LQQ

14 ,

LFQ
8 + LFQ

12 = −LQQ
5 + LQQ

11 ,

2(LFQ
12 − LFQ

13 ) = LQQ
4 − 2LQQ

5 + 2LQQ
11 − 2LQQ

13 − LQQ
14 + 2LQQ

16 ,

2LFQ
14 = LQQ

5 − LQQ
16 ,

2LFQ
15 = LQQ

4 − LQQ
14 ,

LFQ
16 + LFQ

17 = LQQ
9 − LQQ

10 ,

2(LFQ
18 − LFQ

19 ) = −LQQ
11 + LQQ

13 ,

LFQ
18 + LFQ

20 = LQQ
7 − LQQ

10 ,

2(LFQ
20 − LFQ

21 ) = 2LQQ
7 − 2LQQ

8 − 2LQQ
10 + LQQ

11 + 2LQQ
12 ,

2LFQ
22 = LQQ

11 − LQQ
13 . (2.69)

We need one additional relation involving both FF and FDQ:

2(LFF
10 + LFF

12 − LFQ
6 + LFQ

18 ) = LQQ
5 + 2LQQ

8 − LQQ
11 − 4LQQ

12 + LQQ
13 + 2LQQ

15 − LQQ
16 .

(2.70)

These 24 relations are all linearly independent, but they are not independent when
one takes them together with the 8 relations (2.66,2.67) coming from the Bianchi
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identities. In fact the system of all 32 relations has rank 27. This means that one has
50-27=23 independent invariants, in agreement with the counting in section 2.5.3.

One can choose as an independent set the relations (2.68,2.69,2.70), plus the first
three relations in (2.67). Again, there are many ways of solving these relations, but
we shall consider here only two. The first is to retain all the 16 LQQ terms, plus

{LFF
1 , LFF

7 , LFF
16 } and {LFQ

16 , LFQ
18 , LFQ

23 , LFQ
24 } , (2.71)

which is in one-to-one correspondence with the sum of (2.33) and (2.42).
As in the antisymmetric case, one can also keep in the basis the ten LFF invari-

ants

{LFF
1 , LFF

2 , LFF
3 , LFF

7 , LFF
8 , LFF

9 , LFF
10 , LFF

11 , LFF
12 , LFF

16 }

plus

{LQQ
1 , LQQ

10 , LQQ
11 , LQQ

12 , LQQ
14 } and {LFQ

10 , LFQ
11 , LFQ

12 , LFQ
14 , LFQ

16 , LFQ
17 , LFQ

18 , LFQ
23 } .

(2.72)

General MAG á la Cartan

We have listed in (2.51,2.52,2.53,2.54,2.55,2.56) 16 terms of type FF , 38 terms of
type D(T/Q)2 and 45 terms of type FD(T/Q). We thus have 99 quadratic terms,
compared to the 47 ones of the Einstein form of the theory. The next step if to look
for linear relations between these terms. As in the previous sections, these relations
hold up to terms cubic and quartic in F , T , Q.

Multiplying the first Bianchi identity by F we get

LFF
1 − 2LFF

6 = 2LFT
1 + LFT

7 ,

LFF
2 − 2LFF

5 = 2LFT
2 + LFT

5 ,

LFF
3 − LFF

4 + LFF
5 = −LFT

3 + LFT
4 − LFT

6 ,

LFF
7 − LFF

8 + LFF
14 = −LFT

8 + LFT
9 + LFT

17 ,

LFF
11 − LFF

12 + LFF
15 = −LFT

10 + LFT
11 + LFT

18 ,

LFF
13 + 2LFF

14 = −2LFT
12 + LFT

20 , (2.73)

while multiplying it by DT we get

2LFT
1 + LFT

7 = LTT
1 − 2LTT

4 ,

LFT
2 + LFT

3 + LFT
6 = LTT

2 − LTT
5 − LTT

7 ,

2LFT
4 − LFT

5 = −LTT
6 + 2LTT

7 ,

LFT
8 − LFT

9 + LFT
12 = −LTT

3 + LTT
8 + LTT

9 ,

LFT
13 − LFT

14 + LFT
19 = LTT

7 − LTT
8 ,

2LFT
17 + LFT

20 = LTT
6 − 2LTT

8 , (2.74)

and multiplying it by DQ we get

LFQ
1 + LFQ

3 + LFQ
5 = LTQ

1 − LTQ
4 + LTQ

7 ,

LFQ
6 − LFQ

7 + LFQ
14 = −LTQ

2 + LTQ
8 − LTQ

13 ,

LFQ
8 − LFQ

9 + LFQ
15 = −LTQ

3 + LTQ
9 − LTQ

12 ,

LFQ
18 − LFQ

19 + LFQ
22 = LTQ

5 − LTQ
10 + LTQ

11 . (2.75)
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Multiplying the second Bianchi identity by T we get

LFT
5 − 2LFT

14 = 0 ,

LFT
7 − 2LFT

16 = 0 ,

LFT
4 − LFT

13 + LFT
17 = 0 ,

LFT
6 − LFT

15 + LFT
18 = 0 ,

LFT
9 − LFT

11 + LFT
21 = 0 ,

2LFT
19 − LFT

20 = 0 , (2.76)

and multiplying it by Q we get

LFQ
4 − LFQ

16 + LFQ
18 = 0 ,

LFQ
5 − LFQ

17 + LFQ
20 = 0 ,

LFQ
7 − LFQ

11 − LFQ
24 = 0 ,

LFQ
9 − LFQ

13 − LFQ
23 = 0 . (2.77)

In total these are 26 relations, of which 25 are independent. 5 One can obtain an
independent set by eliminating for example the fifth relation in (2.76).

As in the case of symmetric MAG, the Bianchi identities do not exhaust the
set of linear relations between the invariants. The additional ones can be obtained
by the same method that was used for symmetric MAGs, namely using (2.20) and
eliminating terms of the form R2, R∇T and R∇Q from the right hand side. This
gives many additional relations. Considering also these, we have altogether a system
of 70 relations of which 52 are independent. Since the initial number of invariants
is 99, we remain with 47 independent invariants, in agreement with the counting in
the Einstein form of the theory.

In [1] two possible bases were considered. The first consists of all the 38 LTT ,
LQQ and LTQ terms, plus

{LFF
1 , LFF

7 , LFF
16 } and {LFT

13 , LFT
21 } and {LFQ

16 , LFQ
18 , LFQ

23 , LFQ
24 } ,

(2.78)

which is the sum of (2.62) and (2.71), and thus is in one-to-one correspondence with
the sum of (2.33) and (2.50).

Again,it is also possible to choose as a basis all the 16 LFF invariants in (2.51)
plus

{LTT
1 , LTT

2 , LTT
3 , LTT

5 }
{LQQ

1 , LQQ
10 , LQQ

11 , LQQ
12 , LQQ

14 }
{LTQ

1 , LTQ
10 , L

TQ
11 , L

TQ
12 }

{LFT
1 , LFT

8 , LFT
9 , LFT

12 , LFT
13 , LFT

14 , LFT
15 , LFT

18 , LFT
21 }

{LFQ
10 , LFQ

11 , LFQ
12 , LFQ

14 , LFQ
16 , LFQ

17 , LFQ
18 , LFQ

19 , LFQ
23 } . (2.79)

The remaining invariants can be expressed as linear combination of these.

5Twice the first of (2.73), minus the second minus the fourth, minus the second of (2.76), minus
twice the third plus the fifth, is identically zero.
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The bases given for antisymmetric and symmetric MAGs can be obtained from
these by dropping the terms that contain Q and T respectively. In the case of the
first basis this is enough. In the case of the second basis, one has to further eliminate
certain terms of type FF , FDT or FDQ.

2.5.5 Redundant couplings

We have seen how it is possible, using integration by parts and Bianchi identities
(or other relations), to reduce the number of independent invariants that appear in
the quadratic part of the Lagrangian. When dealing with a quantum field theory it
is also possible to reduce the number of independent terms using field redefinitions.
Given a field φ, a general local field redefinition is a transformation

φ′ = φ+ F (φ) , (2.80)

where F depends on φ and its derivatives. A crucial point is that field redefinitions
do not affect the S-matrix. To the concept of field redefinition are linked the notions
of “essential” and “inessential couplings”. If for a coupling ζ we have that

∂S

∂ζ
=

∫
δS

δφ
F (φ) , (2.81)

ζ is said to be “inessential” or “redundant” and it does not enter in the expression
of quantum field theoretic observables. A coupling that does not have this property
is called “essential”.

Let us make the discussion more clear with a concrete example. Given a scalar
field, its kinetic term will be given by 1

2
Z(∂φ)2, where Z is the so-called wave

function renormalization. It turns out that Z is a redundant coupling. Even though
quantum corrections generally change the value of Z, with the redefinition F =
(
√
Z−1)φ we can always set Z = 1. For example, in the Wilsonian renormalization

group, an infinitesimal field redefinition is always performed after an infinitesimal
renormalization group transformation.

When dealing with an EFT there is a criterion to establish what types of trans-
formations F (φ) are admissible [32]. The transformation must involve powers of
the field and its derivatives, since it is local. The simplest transformation is of the
form δφ = αφ, where α is a dimensionless coefficient. The coefficients of all the
other terms will have negative mass dimension and therefore have to be written as
dimensionless numbers times inverse powers of the cutoff Λ. For example, a possible
transformation is given by δφ = (β/Λ2)∂2φ. Applying this transformation to the
mass term m2φ2 we get a contribution δZ = β(m/Λ)2 to the kinetic term. This
change is negligible if the mass is very light compared to the cutoff. Terms with
higher derivatives will appear with in front higher powers on the inverse cutoff and
so they will be even more suppressed. In the same way, terms with higher power of
φ are suppressed. If the theory is renormalizable, one can take Λ → ∞, then the
only allowed transformation is linear in φ and the only redundant coupling is Z.

Let us now specialize this discussion to MAG theories. The couplings ci (in the
Cartan form) or bi (in the Einstein form) multiply the kinetic terms and are akin
to wave function renormalizations, while the couplings ai (in the Cartan form) or
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mi (in the Einstein form) are mass terms. The analogy with the scalar case would
suggest that ci and bi are redundant, but things are more complicated because of
the indices.

This discussion is easier when working with the Einstein form of the theory. We
have two fields, the metric gµν and the distortion ϕαβγ, on which we can perform
transformations. Let us start with the metric and consider redefinitions of the type

δgµν = αgµν + (β1/Λ
2)Rµν + (β2/Λ

2)Rgµν . (2.82)

The redefinition with parameter α does not change the number of derivatives of the
terms it acts on. We are just rescaling the metric and one can use this transformation
to fix the cosmological constant. The redefinitions with parameters β increase the
number of derivatives by two. When applied to the Einstein-Hilbert term, they
change the coefficients bRR

2 , bRR
3 by an amount of order β(mP/Λ)2. Since mP and Λ

are of the same order, this is an allowed transformation and bRR
2 , bRR

3 are redundant
6. Let us now consider redefinitions of the distortion. We need just to consider
redefinitions that are linear in the distortion and either ultralocal (i.e. do not contain
derivatives) or contain two derivatives. The former map mass terms to mass terms
and kinetic terms to kinetic terms; the latter map mass terms to kinetic terms. More
complicated redefinitions will only affect the interaction terms. The linear ultralocal
redefinitions of ϕ are

δϕαβγ = α1ϕαβγ + α2ϕβγα + α3ϕγαβ + α4ϕαγβ + α5ϕγβα + α6ϕβαγ

+gαβ
(
α7tr(12)ϕγ + α8tr(13)ϕγ + α9tr(23)ϕγ

)
+gαγ

(
α10tr(12)ϕβ + α11tr(13)ϕβ + α12tr(23)ϕβ

)
+gβγ

(
α13tr(12)ϕα + α14tr(13)ϕα + α15tr(23)ϕα

)
. (2.83)

To appreciate the power of field redefinitions it is better to focus on an example:
scale-invariant MAG. In this case we cannot have dimension-two terms in the La-
grangian. The 38 × 15 matrix

δbϕϕi
δαj

has rank 15, hence it is possible to use the 15

parameters αj to fix 15 among the bϕϕi . This means that only 23 among the bϕϕi are
essential.

Other redefinitions have to be considered in the general case when all the masses
are of the order of the Planck mass. In this case the only propagating state is
the graviton and it turns out the the only essential coupling is mR. This is due
to the fact that there is a large number of possible field redefinitions. First, there
are 6 redefinitions of the form δϕ ≈ (β/Λ2)∇R (where in the r.h.s. R stands
for the Riemann tensor and two indices are contracted) that can be used to fix
the parameters bRϕ

i . In fact, applied to a mass term, they produce terms of the
form βm/Λ2R∇ϕ, that are unsuppressed since we are assuming that m ≈ Λ2 (the
parameters mi have dimension of mass squared). Then there are 60 transformations
of the form δϕ = (β/Λ2)∇∇ϕ (where in the r.h.s. two indices are contracted) that
can be used to fix all the 38 parameters bϕϕi , since when they are applied to mass
terms produce terms of the form βm/Λ2(∇ϕ)2. Finally, the transformations (2.83)
can be used to fix all the 11 mass terms of ϕ.

6In the perturbative quantization of GR such redefinitions allow to cancel the one-loop diver-
gences [33].
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If some of the masses are much lower than the cutoff, some of these transforma-
tions will be suppressed, and there will remain some essential parameters. This will
have to be discussed on a case by case basis.

2.6 Flat space propagators

2.6.1 Linearized action

As said in the introduction to this Chapter, our aim is to determine which states
propagate when the theory is linearized around flat space and their properties. So
we now consider the linearization of the action around Minkowski space

gµν = ηµν , Aρ
µ
ν = 0 , ϕρ

µ
ν = 0 . (2.84)

The terms in the Lagrangian that contribute at quadratic order in the fluctuation
fields are those that are quadratic in F , T and Q, including also covariant derivatives
of T and Q. In the Cartan form, these are

LC = −1

2

[
− aFF +

∑
i

aTT
i MTT

i +
∑
i

aTQ
i MTQ

i +
∑
i

aQQ
i MQQ

i (2.85)

+
∑
i

cFF
i LFF

i +
∑
i

cFT
i LFT

i +
∑
i

cFQ
i LFQ

i +
∑
i

cTT
i LTT

i +
∑
i

cTQ
i LTQ

i +
∑
i

cQQ
i LQQ

i

]
,

where the first line contains all the dimension-two terms and the second contains
the dimension-four terms. We do not specify the ranges of the sums, because they
depend upon the choice of basis. In the Einstein form, the terms contributing to
the two-point function are

LE = −1

2

[
−mRR +

∑
i

mTT
i MTT

i +
∑
i

mTQ
i MTQ

i +
∑
i

mQQ
i MQQ

i (2.86)

+
∑
i

bRR
i HRR

i +
∑
i

bRT
i HRT

i +
∑
i

bRQ
i HRQ

i +
∑
i

bTT
i HTT

i +
∑
i

bTQ
i HTQ

i +
∑
i

bQQ
i HQQ

i

]
.

The metric fluctuation field is hµν = gµν − ηµν . Since the VEV of A (and ϕ) is
zero, we will not use a different symbol for its fluctuation and identify it with A.
By Poincaré invariance, the quadratic Lagrangian in the Cartan form of the theory,
takes the form

S(2) =
1

2

∫
d4q

(2π)4

(
Aλµν O(AA) τρσ

(C) λµν Aτρσ + 2Aλµν O(Ah) ρσ
(C) λµν hρσ + hµν O(hh) ρσ

(C) µν hρσ

)
,

(2.87)

where, after Fourier transforming, O is constructed only with the metric ηµν and
with momentum qµ. Similarly, in the Einstein form of the theory one obtains

S(2) =
1

2

∫
d4q

(2π)4

(
ϕλµν O(ϕϕ) τρσ

(E) λµν ϕτρσ + 2ϕλµν O(ϕh) ρσ
(E) λµν hρσ + hµν O(hh) ρσ

(E) µν hρσ

)
.

(2.88)
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From (2.15) one finds that

Aλµν = ϕλµν + Jλµν
ρσhρσ , (2.89)

where

Jλµν
ρσ =

i

2

(
qλδ

ρ
µδ

σ
ν + qνδ

ρ
λδ

σ
µ − qµδ

ρ
λδ

σ
ν

)
.

Then we obtain the following relations between the linearized operators in the Cartan
and Einstein formulations:

O(ϕϕ) τρσ
(E) λµν = O(AA) τρσ

(C) λµν ,

O(ϕh) ρσ
(E) λµν = O(Ah) ρσ

(C) λµν + O(AA) ταβ
(C) λµν Jταβ

ρσ ,

O(hh) ρσ
(E) µν = O(hh) ρσ

(C) µν + 2Jλγδ
µνO(Ah) ρσ

(C) λγδ + Jλγδ
µνO(AA) ταβ

(C) λγδ Jταβ
ρσ . (2.90)

2.6.2 Spin Projectors

In this subsection, following the presentation in [2], we are going to introduce the
spin projector formalism, which is useful to analyse the spectrum of operators acting
on multi-index fields in flat space. This formalism allows to decompose the fields in
their irreducible representations under the three-dimensional rotation group. This
can sound complicated, but it is something the reader is probably actually familiar
with. The simplest example of use of the spin-projectors is in fact the decomposition
of a four-vector in its longitudinal and transverse components. Mathematically, a
four vector qa with q2 ̸= 0 breaks SO(1, d−1) to SO(d−1). In physical applications
qa has the meaning of a four-momentum. Given qa, we can decompose every other
vector in parts longitudinal and transverse to it, by using the projectors

q̂a ≡ qa/
√
|q2| , La

b = q̂aq̂
b , Ta

b = δba − Lb
a . (2.91)

Starting from these two basic projectors, that allow to extract the 1− and 0+ com-
ponents of a four-vector, it is possible to build more complicated projectors that
extract the irreducible components under the rotation groups of tensors with more
indices. A general spin-projector will be denoted as Pij(J

P) and it has two sets of
hidden indices: one for the representation JP

i and one for the representation JP
j when

there are multiple representations with same spin and parity. The multi-indices A,
B... consist of either three or two indices, depending whether the carrier field of the
representation is ϕ or h. The spin projectors satisfy the orthonormality relation

Pij(J
P)ABPkl(I

Q)BC = δIJ δPQ δjk Pil(J
P)AC , (2.92)

and the completeness relation ∑
J,P,i

Pii(J
P) = 1 . (2.93)

In the case of two-index tensors one starts dividing the symmetric ones and antisym-
metric ones. These two subspaces of tensors can then be decomposed into irreducible
representations of the rotation group (i.e. in its longitudinal and transverse part in
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each index). The necessary spin projectors [34–36] are probably familiar to the
reader, but we report them anyway. For symmetric rank-2 tensors they are

Ps

(
2+
)
µν

ρσ = T
(ρ
(µT

ρ)
ν) −

1

d− 1
TµνT

ρσ , (2.94)

Ps

(
1−)

µν
ρσ = 2T

(ρ
(µL

ρ)
ν) , (2.95)

Ps

(
0+, ss

)
µν

ρσ =
1

d− 1
TµνT

ρσ , (2.96)

Ps

(
0+, ww

)
µν

ρσ = LµνL
ρσ , (2.97)

Ps

(
0+, sw

)
µν

ρσ =
1√
d− 1

TµνL
ρσ , (2.98)

Ps

(
0+, ws

)
µν

ρσ =
1√
d− 1

LµνT
ρσ , (2.99)

such that

Ps

(
2+
)
µν

ρσ + Ps

(
1−)

µν
ρσ + Ps

(
0+, ss

)
µν

ρσ + Ps

(
0+, ww

)
µν

ρσ = δ
(ρ
(µδ

σ)
ν) . (2.100)

Diagonal terms of projectors between symmetric rank-2 tensors and vectors

Psv

(
1−)

µν
ρ =

√
2

|q|
q(µT

ρ
ν) , (2.101)

Psv

(
0+, sv

)
µν

ρ =
1√
d− 1

qρ

|q|
Tµν , (2.102)

Psv

(
0+, wv

)
µν

ρ =
qρ

|q|
Lµν , (2.103)

For antisymmetric rank-2 tensors

Pa

(
1+
)
µν

ρσ = T
[ρ
[µT

ρ]
ν] , (2.104)

Pa

(
1−)

µν
ρσ = 2T

[ρ
[µL

ρ]
ν] , (2.105)

such that

Pa

(
1+
)
µν

ρσ + Pa

(
1−)

µν
ρσ = δ

[ρ
[µδ

σ]
ν] . (2.106)

Diagonal terms of projectors between antisymmetric rank-2 tensors and symmetric
rank-2 tensors are

Psa

(
1+
)
µν

ρσ = 2T
[ρ
(µL

ρ]
ν) , (2.107)

Pas

(
1+
)
µν

ρσ = 2T
(ρ
[µL

ρ)
ν] . (2.108)

Diagonal terms of projectors between antisymmetric rank-2 tensors and vectors

Pav

(
1−)

µν
ρ =

√
2

|q|
q[µT

ρ
ν] . (2.109)
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s a
TT 2+

4 , 0+
5 1+

4

TL 1−
7 1−

8

LL 0+
6 -

Table 2.1: SO(3) spin content of projection operators for a two-index tensor in d = 4
(s=symmetric, a=antisymmetric).

The representations of O(3) are labelled by spin and parity, and they are listed in
Table 2.1.

Here the subscript distinguishes different instances of the same representation.
These representations arise as perturbations of the tetrad. If one works only with
the metric, the antisymmetric parts can be dropped.

In the case of three-index tensors, as one could expect, the algebra is quite more
complicated and the complete procedure for the construction of spin-projectors for
three-index tensors was carried out only recently in [2, 37]

Let us now show the step of this procedure. Let us consider three-index tensors
as representations of GL(d). In order to discuss their symmetry properties, we will
focus on the second pair of indices, hence when we say that tcab is (anti)symmetric,
without further specification, we mean tcba = ∓tcab.

The space V of three-index tensors is a vector space of dimension d3. This space
admits two invariants subspaces: the subspace V (s) of symmetric tensors and the
subspace V (a) of antisymmetric tensors. The dimensions of these two subspaces are
d2(d+ 1)/2 and d2(d− 1)/2 respectively. As first ingredients in our constructions of
the spin projectors we need the projectors onto these subspaces, namely

Π
(s)
cab

def =
1

2
δdc

(
δeaδ

f
b + δfaδ

e
b

)
, Π

(a)
cab

def =
1

2
δdc

(
δeaδ

f
b − δfaδ

e
b

)
. (2.110)

Inside these two subspaces we can identify two other invariant subspaces: the sub-
space V (ts) of totally symmetric tensors, of dimension d(d + 1)(d + 2)/6, and the
subspace V (ta) of totally antisymmetric tensors, of dimension d(d− 1)(d− 2)/6. We
can now define the projectors

Π
(ts)
cab

def =
1

6

(
δdc δ

e
aδ

f
b + δdc δ

f
aδ

e
b + δfc δ

d
aδ

e
b + δfc δ

e
aδ

d
b + δecδ

f
aδ

d
b + δecδ

d
aδ

f
b

)
,

(2.111)

Π
(ta)
cab

def =
1

6

(
δdc δ

e
aδ

f
b − δdc δ

f
aδ

e
b + δfc δ

d
aδ

e
b − δfc δ

e
aδ

d
b + δecδ

f
aδ

d
b − δecδ

d
aδ

f
b

)
.(2.112)

which extract the totally symmetric and totally antisymmetric components of any
given tensor. The complement of V (ts) in V (s) and of V (ta) in V (a) are also invari-
ant subspaces and wil be denoted as V (hs) and V (ha) respectively. Here “hs” and
“ha” stand for “hook-symmetric” and “hook-antisymmetric”. These tensors are
(anti)symmetric but have zero totally (anti)symmetric part. Note that V (hs) and
V (ha) have the same dimension. Of course, we can also define the projectors onto
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such subspaces, which read

Π
(hs)
cab

def = Π
(s)
cab

def − Π
(ts)
cab

def =
1

6

(
2δdc δ

e
aδ

f
b − δdb δ

e
cδ

f
a − δdaδ

e
bδ

f
c

)
+ (a ↔ b) ,

(2.113)

Π
(ha)
cab

def = Π
(a)
cab

def − Π
(ta)
cab

def =
1

6

(
2δdc δ

e
aδ

f
b − δdb δ

e
cδ

f
a − δdaδ

e
bδ

f
c

)
− (a ↔ b) ,(2.114)

With all these preliminaries, given a three-index tensor we can decompose it in its
GL(d)-irreducible components as

tcab = t
(ts)
cab + t

(hs)
cab + t

(ha)
cab + t

(ta)
cab . (2.115)

where

t
(ts)
cab =

1

6
(tcab + tcba + tbca + tbac + tabc + tacb) ,

(2.116)

t
(hs)
cab =

1

6
(2tcab + 2tcba − tacb − tabc − tbca − tbac) ,

(2.117)

t
(ha)
cab =

1

6
(2tcab − 2tcba + tacb − tabc − tbca + tbac) ,

(2.118)

t
(ta)
cab =

1

6
(tcab − tcba + tbca − tbac + tabc − tacb) . (2.119)

It is now possible to decompose V into irreps of SO(d − 1). The first step is to
rewrite the identity in a rather fancy way:

δdc δ
e
aδ

f
b = (T d

c + Ld
c)(T

e
a + Le

a)(T
f
b + Lf

b ) (2.120)

With some algebra it is possible to see that the combinations

TTT ; TTL+ TLT + LTT , TLL+ LTL+ LLT , LLL (2.121)

(all with fixed indices) are projectors. The next step is to consider the simultaneous
eigenspaces with eigenvalue 1 of these and of the GL(d) projectors introduced above.
The dimensions of these spaces are reported in Table 2.2. The last column and the
last row give the total dimension of the +1 eigenspaces of the projectors in the
corresponding rows and columns.

The next step is to decompose these subspaces in irreducible representations of
SO(d − 1). At this point there is one non-trivial step, namely observing that the
hs- and ha-projections of 3

2
LTT and TTL + TLT − 1

2
LTT are themselves projec-

tors. Using this result and isolating the “trace” and the “tracefree” part of each
representation one can obtain the irreducible representations of SO(d− 1). For the
case of d = 4, the SO(3) irreducible representations are listed in Table 2.3, together
with the spin and parity carried by them. The subscripts refer to the number in the
labelling of the projectors.
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ts hs ha ta dim

TTT d(d2−1)
6

d(d−1)(d−2)
3

d(d−1)(d−2)
3

(d−3)(d−2)(d−1)
6

(d− 1)3

TTL+ TLT + LTT d(d−1)
2

(d− 1)2 (d− 1)2 (d−2)(d−1)
2

3(d− 1)2

LLT + LTL+ TLL d− 1 d− 1 d− 1 0 3(d− 1)
LLL 1 0 0 0 1

dim d(d+1)(d+2)
6

d(d2−1)
3

d(d2−1)
3

d(d−1)(d−2)
6

d3

Table 2.2: Dimensions of projected spaces in d dimensions.

ts hs ha ta
TTT 3−, 1−

1 2−
1 , 1−

2 2−
2 , 1−

3 0−

TTL+ TLT + LTT 2+
1 , 0+

1 - - 1+
3

3
2
LTT - 2+

2 , 0+
2 1+

2 , -
TTL+ TLT − 1

2
LTT - 1+

1 2+
3 , 0+

3 -
TLL+ LTL+ LLT 1−

4 1−
5 1−

6 -
LLL 0+

4 - - -

Table 2.3: SO(3) spin content of projection operators for ϕ in d = 4. (ts/ta=totally
(anti)symmetric; hs/ha=hook (anti)symmetric

Let us make the reader notice that each representation of the group SO(3) may
appear more than once in the decomposition of Acab. To distinguish these copies
we will use the label i. For example the representation 2− occurs twice, and so we
will call these two instances 2−

1 and 2−
2 . To make things even more confusing, the

same representation may occur also in the decomposition of the two-tensor hab. We
use the same label for all these representations. As an example let us consider the
representation 2+, that occurs a grand total of four times: the representations 2+

i

with i = 1, 2, 3 come from Acab whereas 2+
4 comes from hab.

Let us now stress that there are two types of spin projectors. To each represen-
tation JP

i is associated a properly called spin projector, denoted Pii(J
P). Then, for

each pair of representations with the same spin-parity, labelled by i, j, there is a
so-called intertwining operator Pij(J

P). For the sake of simplicity we will refer to
all the projectors and intertwiners as the “spin-projectors”.

To end this subsection let us remind the reader that these spin projectors are suit-
able to decompose tensors that either have no symmetry property or are (anti)symmetric
in the last two indices. If one wants to consider tensors that are (anti)symmetric in
the first and third index, it is better to work with a different set of spin projectors
P ′
ij(J

P), such that whenever the representation i or j is carried by a three-index
tensor, the first two indices are permuted. For example

P ′
11(2

+)cabdef = P11(2
+)acbedf , P ′

14(2
+)cabef = P14(2

+)acbef etc . (2.122)

With the same reasoning it is possible to obtain the suitable spin projectors for
tensors that are (anti)symmetric in the first two indices.

We can now go back to the quadratic action and rewrite it in a more useful form
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using the orthogonality and completeness properties of the spin projectors:

S(2) =
1

2

∫
d4q

(2π)4

∑
JPij

Φ(−q) · aij(JP)Pij(J
P) · Φ(q) , (2.123)

where Φ = (A, h) in Cartan form and Φ = (ϕ, h) in Einstein form, the dot implies
contraction of all indices as appropriate and aij(J

P ) are matrices of coefficients. For
example, the A− A part of (2.87) is

1

2

∫
d4q

(2π)4

∑
JPij

aij(J
P)AλµνPij(J

P)λµν
τρσAτρσ ,

with the sums running over all the representations listed in the preceding table.
When both representations JP

i and JP
j are carried by A, the matrix elements

aij(J
P) can be obtained in the following way:

aij(J
P) =

1

d(JP)
Pij(J

P)cabdefOdef
AAcab

(2.124)

=
1

d(JP)
Pki(J

P)cabdef Odef
AAℓmn Pjk(JP)ℓmn

cab , (2.125)

for any fixed k, and where d(JP) is the dimension of the representation JP . The
second equality follows from (2.92), and it proves that it suffices to know the projec-
tions operators Pjk for any fixed k in order to obtain all coefficients matrices. This
was also observed in [38], where Pjk for a fixed k ( chosen for convenience to give
the simplest projector) were referred to as “semi-projectors”. In a similar way, if
the representation JP

i is carried by A and JP
j is carried by h, we can write

aij(J
P) =

1

d(JP)
Pij(J

P)decabOcab
Ahde

(2.126)

=
1

d(JP)
Pki(J

P)cabdef Odef
Ah mn Pjk(JP)mn

cab , (2.127)

where we have chosen k that is carried by A. These matrices aij(J
P) will be called

“coefficient matrices”.

2.6.3 Gauge invariance

An important next step in our discussion is understanding in which way gauge
invariances manifest in the spin projectors formalism. To this aim, let us introduce
sources for our fields:

JA =

(
τcab
σab

)
. (2.128)
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The linearized action with source term can be written

S(2) =

∫
ddq

[
1

2

∑
JPij

Φ(−q) · aij(JP)Pij(J
P) · Φ(q) + J (−q) · Φ(q)

]
, (2.129)

which gives the field equations∑
JPij

aij(J
P)Pij(J

P) · Φ = −J . (2.130)

We can invert these equations and obtain Φ as a function of J . Plugging this result
into S(2) we obtain a quadratic form in J : the saturated propagator Π. Now it is
the moment in which gauge invariances come into play: they correspond to possible
null eigenvectors of the matrix aij in a given spin-parity sector. To understand the
reason for this let us suppose that, for a given JP , the n×n matrix aij has rank m,
hence it admits (n−m) null vectors,∑

j

aijV
(r)
j = 0 , i, j = 1, ..., n, r = 1, ..., n−m , (2.131)

Then it is immediate to see that (2.129) is invariant under the transformation

δΦ =
∑
k,r

V
(r)
k Pkℓ · ξ(r) , ∀ ℓ , (2.132)

where ξ(r) are arbitrary functions of the coordinates, provided that the sources obey
the constraints ∑

i

V
†(r)
i Pji · J = 0 , ∀ j, r, J,P , (2.133)

In principle this analysis has to be repeated in each spin sector to determine all the
gauge symmetries and source constraints. In practice this cumbersome procedure
will not be necessary. In fact gauge symmetries can be divided in two categories:
the symmetries that are already present in the original action and the so-called
“accidental” symmetries that are only present in the linearized action. The latter are
broken by interactions and therefore cannot be maintained in the quantum theory. In
the following we will consider only theories that do not have accidental symmetries.
Having decided to not consider accidental symmetries, the only infinitesimal gauge
invariance is the diffeomorphisms invariance7, that at the linearized level implies the
invariance under the transformations

δAcab = −qbqcξa , δhab = i(qaξb + qbξa) . (2.134)

Schematically we can write this as δΦ = Dξ. Now we observe that, being Dξ a null
eigenvector of the linearized kinetic term, we must have∑

JPij

aij(J
P)Pij(J

P)Dξ = 0 . (2.135)

7This is true since we work with coordinate bases. With other bases, there would be additional
gauge invariances.
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An explicit computation shows that Pij(J
P)Dξ is only nonzero for JP = 1− and

j = 4, 5, 6, 7 or JP = 0+ and j = 4, 6. Then one finds that both a(1−) and a(0+)
have a null eigenvector. This lowers the ranks of these matrices, with a(1−) having
rank 6 and a(0+) having rank 5. Since also the source term has to be invariant
under this symmetry we have one so-called source constraint:

2iqaσac + qaqbτbca = 0 . (2.136)

Gauge fixing is simply obtained taking the inverse of any m×m submatrix of aij with
nonzero determinant. In this way it is possible to write the propagator sandwiched
between physical sources [39]. Let us call bkℓ, (k, ℓ = 1, ...m), this submatrix. The
resulting saturated propagator Π is

Π = −1

2

∑
J,P,k,ℓ

b−1
kℓ (JP)J † · Pkℓ(J

P) · J (2.137)

Let us remind that in our notation b−1
kℓ denotes the matrix element of b−1 in the

representations k, ℓ, which need not agree with the element of the matrix b−1 in the
k-th row and ℓ-th column (unless a is non-degenerate, in which case b = a). Now let
us observe that since bij(q) is a Hermitian matrix and its momentum dependence is
polynomial, the poles at non-vanishing values of q2 can only come from detb(JP).
Let us assume that for each given JP there are s propagating particles, with s ≤ m.
Then we have

det b = C(q2 +m2
1) · · · (q2 +m2

s) , (2.138)

where (C,m2
1, . . . ,m

2
s) are constants. For a physically sensible spectrum these con-

stants must be real and we will further assume that the masses m2
n, n = 1, ..., s, are

non-vanishing and distinct (possibly, one of the masses could be zero). The deter-
minant detb has a simple zero for q2 = −m2

n, so exactly one eigenvalue of b must
have a zero there. This implies an important result: the residue matrix

lim
q2→−m2

n

(q2 +m2
n)b−1 (2.139)

has exactly one non-vanishing eigenvalue. This will be important when discussing
the condition for ghost-freedom.

However, before discussing this condition and the one for tachyon-freedom we
need to address one final issue. In is important to note that the spin projectors in
(2.137) contain powers of 1/q2 that do not contribute to the physical propagators.
These are spurious poles at zero momentum, that we will call kinematical singular-
ities. These spurious poles cancel out in the full saturated propagator. These poles
arise from the product of constants, or 1/(q2 + m2), with the longitudinal parts of
the spin projection operators. In the latter case, a partial fraction decomposition
gives rise to terms in which the spin projection operators are evaluated on the mass
shell, plus terms with powers of 1/q2. For example:

1/q2

q2 +m2
=

1/(−m2)

q2 +m2
+

1/m2

q2
, (2.140)
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and similarly for expressions of the form 1/((q2)n(q2 + m2)). The first term on the
r.h.s. has the same pole at q2 = −m2, but in its coefficient the momentum squared
is now evaluated at the pole. The second term gives another spurious pole at zero.
In the end all the spurious poles cancel out and the final result is a combination
of the spin projectors evaluated on the mass shell or constants sandwiched between
sources that obey source constraints.

2.6.4 Conditions for tachyon- and ghost-freedom

Having discussed the problem of kinematical singularities, we can turn to the con-
ditions for the absence of ghosts and tachyons. Let us start with the obvious one,
the tachyon-freedom condition, namely

Tachyon-free =⇒ m2
n > 0 , n = 1, ..., s . (2.141)

The condition for ghost-freedom is trickier than it seems. To start, let us consider
the case of a scalar field: in this case the coefficient matrix a is just

a = −q2 −m2 , (2.142)

and must have m2 > 0 in order not to have a tachyon. The corresponding saturated
propagator, obtained by solving the classical equation of motion for the source and
inserting back in the linearized action, is

Π =
1

2

∫
d4q

(2π)4
J(−q) 1

q2 +m2
J(q) . (2.143)

When the source is a more complicated tensor, there could be −1 factor depending
on the the way the indices are contracted. For example, in

Π =
1

2

∫
d4q

(2π)4
Jαβγ(−q) 1

q2 +m2
Pαβγ

λµνηλρηµσηντJ
ρστ (q) , (2.144)

whenever one of the indices of the projector P is associated to a longitudinal projec-
tor, the corresponding metric gives −1. The reason for this is that in the rest frame
where the four-momentum takes the form qµ = (m, 0, 0, 0) the longitudinal projector
is equal to 1 only in the time-time (0, 0) component, while the transverse projector
is equal to 1 only in the spatial (i, j) components. Hence there is an overall −1
factor whenever the projector P contains an odd number of longitudinal projectors.

Let us now express this fact in a more formal way. To start, let us diagonalize
the matrix b−1 using a unitary matrix U : Ub−1U † = D, with Dij = λiδij. Now the
saturated propagator reads

Π = −1

2

∑
J,P,i,j,k

λk U
†
ikUkj J † · Pij · J . (2.145)

where we have suppressed the JP labels to simplify the notation. Now it is possible
to define

Ĵ = UijPij · J , (2.146)

38



and thanks to the orthonormality property of the spin projectors, one obtains [17]

Π = −1

2

∑
J,P,k

λk Ĵ · Pkk · Ĵ . (2.147)

We know that only one eigenvalue has nonzero residue at a given pole. The condition
for ghost-freedom is that the residue of Π at a given pole must be positive. Since
on-shell

Tab

∣∣∣
q2=−m2

= δaiδbj , Lab

∣∣∣
q2=−m2

= −δa0δb0 , i = 1, 2, 3 , (2.148)

we can write the ghost-free condition as

Ghost-free =⇒ Res
q2=−m2

n

s∑
k=1

[
b−1
kk (JP)(−1)nL(k)+1

]
> 0 , ∀J,P , n , (2.149)

where nL(k) is the number of L factors in Pkk(JP).8.

To conclude this section, let us note that in any J P sector involving the matrix
b−1 with rank greater than one, there will be mixing of sources that survive the
source constraints. All the kinematical singularities must cancel and the result for
the saturated propagator in such JP sectors can be written in the standard form
of the spin JP propagators, with a suitable combination of these sources. This
phenomenon will be clearly shown in the next Chapter. For convenience, we present
in the Appendix A the standard propagators of fields of spin 0+, 0−, 1+, 1−, 2+, 2−

and 3−.

2.7 Example of MAG with dimension-two terms

only

Let us now see a practical application of all this machinery in the case of MAGs.
In this section we are going to analyze a famous example of MAG theory, namely
Weitzenböck theory, also known as antysymmetric teleparallel theory. In this theory
F = 0 and Q = 0, and the action is quadratic in torsion

S = −1

2

∫
d4x
√

|g|
[
aTT
1 TµρνT

µρν + aTT
2 TµρνT

µνρ + aTT
3 tr(12)Tµtr(12)T

µ
]
. (2.150)

The condition F = 0 implies

Aν
ρ
σ =

(
Λ−1

)ρ
α∂νΛα

σ , (2.151)

8In a convention where ηab = diag(+−−−), the signs in (2.148) are reversed, and the grading
is given by the number nT (k) of T factors in Pkk(J

P). This number, mod 2 , is the same in
any JP sector, hence the ghost-free condition becomes Res

q2=−m2
k

tr
[
−b−1(JP)(−1)P

]
> 0, in any JP

sector, where tr is the ordinary trace.
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When we linearize the theory around flat spacetime this conditon becomes Aµ
ρ
ν =

∂µλ
ρ
ν , where Λρ

σ = δρσ +λρσ. The condition Q = 0 implies that Aµρν +Aµνρ = ∂µhρν
. Combining these results we have

Aµρν =
1

2
∂µhρν + ∂µΩρν , (2.152)

whit Ω being the antisymmetric part of λ. The action now reads

S = −1

2

∫
d4q

(2π)4

[
− (2aTT

1 + aTT
2 )

4
q2hµνh

µν +
(2aTT

1 + aTT
2 − aTT

3 )

4
qµqλh

µνhλν

+
aTT
3

2
qµqνh

µνh− aTT
3

4
q2h2 − (2aTT

1 − aTT
2 )q2ΩµνΩµν

+(2aTT
1 − 3aTT

2 − aTT
3 )qµqλΩµνΩλ

ν − (2aTT
1 + aTT

2 + aTT
3 )qµqλΩµνhλν

]
.

The action can be rewritten in a form such as (2.123):

S =
1

2

∑
P,i,j

∫
d4q

(2π)4
(Ω(−q) h(−q)) ·

(
aΩΩ
ij P

ΩΩ
ij aΩh

ij P
Ωh
ij

ahΩij P
hΩ
ij ahhij P

hh
ij

)
·
(

Ω(q)
h(q)

)
+

∫
d4q

(2π)4
{σ(−q) · h(q) + τ(−q) · Ω(q)} , (2.153)

where

a
(
2+
)

=
(2aTT

1 + aTT
2 )

4
q2 , (2.154a)

a
(
1+
)

=
(
2aTT

1 − aTT
2

)
q2 , (2.154b)

a
(
1−) =

aTT
4

8
q2
(

4 −2
−2 1

)
, (2.154c)

a
(
0+
)

=
(aTT

4 + 2aTT
3 )

4
q2
(

1 0
0 0

)
, (2.154d)

with

aTT
4 ≡ 2aTT

1 + aTT
2 + aTT

3 , (2.155)

The order of the rows and columns in the 1− sector is (Ω, h). The matrices a (1−) and
a (0+) have rank 1, as expected since the theory is invariant under diffeomorphisms.
To fix the gauge we just have to remove the second row and column. A linearized
diffeomorphism transformation reads

hµν → hµν + ∂µξν + ∂νξµ , (2.156a)

Ωµν → Ωµν −
1

2
∂µξν +

1

2
∂νξµ , (2.156b)

Note that the transformation of Ω is just a consequence of the transformation laws of
A and h and formula (2.152) The source constraint due to diffeomorphism invariance
is

−2qµσµν + qµτµν = 0 . (2.157)
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The saturated propagator is

Π = −1

2

∫
d4q

(2π)4

{
4

(2aTT
1 + aTT

2 )q2

[
σµνσ

µν − aTT
3

2aTT
1 + aTT

2 + 3aTT
3

(
σµ
µ

)2]
(2.158)

+
1

(2aTT
1 − aTT

2 )q2

[
τµντ

µν − 4(aTT 2
2 + 2aTT

1 aTT
2 + 2aTT

1 aTT
3 )

(2aTT
1 + aTT

2 )(2aTT
1 + aTT

2 + aTT
3 )

qµqν

q2
τµρτν

ρ

]}
.

To make this propagator more clear it is convenient to perform the redefinitions

σ̃µν ≡ σµν + C σρ
ρ ηµν , (2.159a)

τµν ≡ − i

q2
(qµχν − qνχµ) + τ̃µν with qµχµ = qµτ̃µν = 0 , (2.159b)

Tuning the parameter C , the saturated propagator can be rewritten as

Π = −1

2

∫
d4q

(2π)4

[
4

(2aTT
1 + aTT

2 )q2

(
σ̃µν σ̃

µν − 1

2

(
σ̃µ
µ

)2)
(2.160)

+
1

(2aTT
1 − aTT

2 )q2
τ̃µν τ̃

µν − 2(2aTT
1 + aTT

2 − aTT
3 )

(2aTT
1 + aTT

2 )(2aTT
1 + aTT

2 + aTT
3 )q4

χµχ
µ

]
.

Now it is immediate to recognize the usual graviton in the first term, while the
second term correspond to a massless spin 1+ state and the last to a dipole ghost
with spin 1−.

The latter is pathological and in order to eliminate it, we have to impose

aTT
4 = 0 . (2.161)

With this constraint, we remain with linearized GR with in addition a spin 1+

particle. Imposing 2aTT
1 − aTT

2 > 0 the propagator of the latter assumes the proper
form (A.29). Let us note that this theory is equipped with two gauge invariances.
One is, of course, diffeomorphism invariance. The second one is the invariance under

Ωµν → Ωµν + ∂µχν − ∂νχµ . (2.162)

This gauge invariance is the reason why the additional degree of freedom is massless.
The propagation of this state can be eliminated imposing

2aTT
1 − aTT

2 = 0 , (2.163)

With this assumption Ω is a pure degree of freedom and completely disappears from
the action. What we remain with is just the antisymmetric teleparallel equivalent
of the Hilbert action.

In this example we have seen how, starting from a given Lagrangian, we can
determine the particle spectrum of the theory. In the next Chapter we will perform
the inverse operation, namely we will decide which particle we want to propagate and
we will use the spin projectors formalism to perform a retro-engineering operation
and obtain the relations that the parameters in the Lagrangian have to satisfy to
propagate this coveted particle (together with the graviton).
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Chapter 3

Some simple MAGs with
propagating torsion

In this Chapter we want to focus on antisymmetric MAGs, so theories which are
metric-compatible, but with a non-vanishing torsion. We want to construct the-
ories which propagate the standard massless graviton and a healthy particle with
assigned spin and parity when linearized around flat spacetime. The basis of in-
variant we use to build the Lagrangian is the one listed in the previous Chapter.
Let us stress that we include terms of the form (∇T )2, that were not considered in
the previous literature. Moreover, since we are interested in building theories which
propagate healthy particles we will not consider terms of the form R2, since they are
notoriously cause of ghosts (even though the question is not yet settled [40–45]).1

To simplify the search we will impose additional kinematical constraints on torsion,
and assume that it is either totally antisymmetric or hook-antisymmetric (i.e. its
totally antisymetric part vanishes). As we have discussed in the previous Chapter
these are invariant subspaces under the action of the group GL(4). The correspond-
ing degrees of freedom can be read from Table 2.3. We shall return later to the
general antisymmetric MAG. We will further assume that all the non-propagating
degrees of freedom have non-vanishing masses, so that we can avoid the problems
due to accidental gauge symmetries. The only gauge symmetry that we assume is
diffeomorphism invariance, that enforces

a(1−)i7 = a(1−)7i = 0 , a(0+)i6 = a(0+)6i = 0 . (3.1)

One can fix the gauge redundancy by simply suppressing these rows and columns.
We report in Appendix B the explicit formulae for the coefficient matrices and in
Appendix C the map for going from Einstein form to Cartan form.

3.1 Totally antisymmetric case

The totally antisymmetric part of torsion consists of the states 1+
3 and 0−. In the

Lagrangian we impose total antisymmetry of torsion as a kinematical constraint.

1Actually it was showed in [46] that allowing the propagation of some torsional degrees of
freedom it is possible to avoid ghosts and tachyons also in presence of these terms.
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In this case MTT
2 = −MTT

1 , MTT
3 = HTT

3 = HTT
8 = HTT

9 = 0, HTT
2 becomes

proportional to HTT
1 , and HTT

5 , HTT
6 , HTT

7 become proportional to HTT
4 . Thus we

can set

mTT
2 = 0 , bTT

2 = bTT
5 = bTT

6 = bTT
7 = 0 , (3.2)

without loss of generality, and keep only MTT
1 , HTT

1 , HTT
4 as independent invariants.

The only parts of the coefficient matrices to be considered are:

b(2+) ≡ a(2+)44 =
1

4

2

(−q2) , (3.3)

b(1+) ≡ a(1+)33 = 4

(
bTT
1 +

1

3
bTT
4

)
(−q2) − 4mTT

1 , (3.4)

b(1−) ≡ a(1−)77 = 0 , (3.5)

b(0+) ≡ a(0+){5,5} = −1

2

2

(−q2) , (3.6)

b(0−) ≡ a(0−) = 4bTT
1 (−q2) − 4mTT

1 . (3.7)

The matrices 2+, 1− and 0+ are exactly as in pure GR, and the remaining two are
the potentially propagating new degrees of freedom. Since there is only one state
for each spin/parity, the analysis is particularly simple.

If we want only 1+ to propagate, we have to set to zero the coefficient of q2 in
b(0−), which implies bTT

1 = 0. This leaves us with

b(1+) =
4

3

(
−bTT

4 q2 − 3mTT
1

)
. (3.8)

Since the spin projector P (1+) is of the form TTL, we have an additonal minus sign.
We can now state the conditions for the 1+ state to have a healthy propagation:

bTT
4 < 0 , mTT

1 < 0 . (3.9)

Similarly, if we want only 0− to propagate, we have to impose bTT
4 = −3bTT

1 . In
this case there is no additional minus sign since the spin projector P (0−) is of the
form TTT . Hence the conditions for a healthy propagation of 0− are immediately
obvious from the form of b(0−):

bTT
1 > 0 , mTT

1 > 0 . (3.10)

As a last remark, if we allow both degrees of freedom to propagate, it is impossible
to prevent one of them from being a ghost or tachyon.

Checking the result: axial vector torsion

These conditions become more clear if one identifies the 1+
3 and 0− degrees of freedom

as the transverse and longitudinal components of an axial vector vµ, dual to the
torsion tensor [47]:

Tαβγ = ηαβγδv
δ , (3.11)
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where ηαβγδ is the totally antisymmetric tensor. In such a case the Lagrangian can
be rewritten as

LE = (3bTT
1 + bTT

4 )∇µvν∇µvν − bTT
4 ∇µvν∇νvµ + 3mTT

1 vµv
µ . (3.12)

Setting

bTT
1 = 0 , bTT

4 = −1

2
, mTT

1 = −1

6
m2 , (3.13)

the Lagrangian (3.12) becomes the Proca Lagrangian that correctly describes a
massive spin-1 state, whereas for mTT

1 = 0 it becomes the Maxwell Lagrangian that
correctly describes a massless spin-one state. This confirms the signs of (3.9). Note
that in the massless case we have b(0−) = 0, which is a symptom of the abelian
gauge invariance of the theory. This is a genuine gauge symmetry of the full action,
not an accidental one.

On the other hand, in order to have only the 0− propagating, we eliminate the
first term in Equation (3.12) by setting bTT

4 = −3bTT
1 and integrate by parts twice,

so that the Lagrangian becomes

LE = 3
(
bTT
1 (∇µv

µ)2 +mTT
1 vµv

µ
)
. (3.14)

If we decompose v in its transverse and longitudinal parts

vµ = vTµ + ∇µψ , (3.15)

the transverse part is seen not to propagate, whereas for the longitudinal one we
remain with

LE = 3ψ2(bTT
1 2−mTT

1 )ψ . (3.16)

Defining scalars ψ1 and ψ2 through

ψ1 =
1

mTT
1

(bTT
1 2−mTT

1 )ψ , ψ2 =
1

mTT
1

bTT
1 2ψ , (3.17)

the Lagrangian can be rewritten as

LE = −3mTT
1 ψ12ψ1 + 3

mTT
1

bTT
1

ψ2(b
TT
1 2−mTT

1 )ψ2 , (3.18)

that indicates the presence of two propagating scalars. However, the massless scalar
is a pure gauge degree of freedom, because the Lagrangian (3.16) is invariant under
the shift ψ → ψ + ξ with 2ξ = 0 and only ψ1 is affected by the shift. Thus there is
only one massive scalar, and (3.10) are the correct conditions for it not to be a ghost
or tachyon. See [48] for a recent discussion of the appearance of (3.14) in higher
derivative gravity.
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3.2 Hook-antisymmetric case

We can now turn to the hook-antisymmetric case. Since in this case the totally
antisymmetric part of T vanishes, we have to impose

T abc = T acb + T bac . (3.19)

This identifies some operators in the Lagrangian with others as

MTT
2 =

1

2
MTT

1 , HTT
2 =

1

2
HTT

1 , HTT
5 = HTT

4 −HTT
7 , HTT

6 = 2HTT
7 . (3.20)

As a consequence, we can set

mTT
2 = bTT

2 = bTT
5 = bTT

6 = 0 , (3.21)

without loss of generality and the Lagrangian simplifies to

LE = −1

2
mTT

1 MTT
1 − 1

2
mTT

3 MTT
3 − 1

2
bTT
1 HTT

1 − 1

2
bTT
3 HTT

3 − 1

2
bTT
4 HTT

4

−1

2
bTT
7 HTT

7 − 1

2
bTT
8 HTT

8 − 1

2
bTT
9 HTT

9 − 1

2
bRT
3 HRT

3 − 1

2
bRT
5 HRT

3 . (3.22)

We choose the nondegenerate b-matrices as

b(2+) = a(2+){3,4},{3,4} , b(1−) = a(1−){3,6},{3,6} , b(0+) = a(0+){3,5},{3,5} .
(3.23)

Then, the nondegenerate coefficient matrix for

b(2+)=
(
−mTT

1 − 1
2
(2bTT

1 + bTT
4 )q2 i

bRT
3

4
√
2
q3 − i

bRT
3

4
√
2
q3 −m2

P

4
q2
)
, (3.24)

b(2−)=−(mTT
1 + bTT

1 q2) , (3.25)

b(1+)=−mTT
1 − 1

6
(6bTT

1 + bTT
4 + 2bTT

7 )q2 , (3.26)

b(1−)=

(
−mTT

1 −mTT
3 − (bTT

1 + bTT
3 )q2 − 1

2
√
2
[2mTT

3 + (2bTT
3 + bTT

8 )q2]

− 1
2
√
2
[2mTT

3 + (2bTT
3 + bTT

8 )q2] −1
2(2m

TT
1 +mTT

3 )− 1
2(2b

TT
1 + bTT

3 + bTT
4 + bTT

7 + bTT
8 )q2

)
,

(3.27)

b(0+)=

(
−1

2
(2mTT

1 + 3mTT
3 ) − 1

2
(2bTT

1 + 3bTT
3 + bTT

4 + 3bTT
9 )q2 i

bRT
3 +6bRT

5

4
√
2

q3

−i b
RT
3 +6bRT

5

4
√
2

q3
2

2
q2

)
.

(3.28)

Also in this case our desire is to propagate another state on top of the graviton. The
determinants of the coefficient matrices for 2+ (3.24) and 0+ (3.28) contain terms
of order q6 coming from their off-diagonal parts. This indicates that the mixing
of torsion and graviton fluctuation would lead to the propagation of an additional
degree of freedom. For our aims we can therefore simplify the analysis by setting
bRT
3 = bRT

5 = 0. In this way the graviton is completely decoupled from torsion at
quadratic level.
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Propagating graviton and massive 2+

To prevent the propagation of 2− we set bTT
1 = 0, and to prevent the propagation

of 1+ we set bTT
7 = −bTT

4 /2. In order for the torsional 2+ state to be a propagating
massive degree of freedom, we must then have mTT

1 ̸= 0 and bTT
4 ̸= 0, which we

assume in the following. Then, we must remove the terms of order q4 and q2 from
the determinant of b(1−) and the term of order q2 in the (1, 1)-entry of b(0+). These
conditions admit the solution

mTT
3 = − mTT

1

(bTT
4 )

2

[(
bTT
4

)2
+ 2bTT

4 bTT
8 + 3

(
bTT
8

)2]
,

bTT
3 =

(
bTT
8

)2
2bTT

4

, bTT
9 = −

2
(
bTT
4

)2
+ 3

(
bTT
8

)2
6bTT

4

. (3.29)

With this parametrization the coefficient matrix is reduced to

b(2+) =
1

2

(
−bTT

4 q2 − 2mTT
1

)
. (3.30)

Now recalling that the spin projector P (2+)33 is of type TTL, the propagator has
an additional minus sign, so that the ghost- and tachyon-free conditions are

bTT
4 < 0 , mTT

1 < 0 . (3.31)

As a check, we can now insert (3.29) and the other conditions on the coefficients in
the saturated propagator (2.123) and use the explicit form of the spin projectors. In
principle the resulting expression could contain terms up to q−8 (with two powers
coming from the kinetic coefficients and six from the spin projectors) but all terms
with 8, 6 and 4 inverse powers of q duly cancel, and we remain with

Π = Πgrav + Πmassive + (rest) , (3.32)

where

Πgrav =
2
2

∫
d4q

(2π)4
σµν(−q) 1

q2

(
Ps(2

+)µνρλ −
1

2
Ps(0

+, ss)µνρλ

)
σρλ(q)

=
2
2

∫
d4q

(2π)4
σµν(−q) 1

q2

(
ηµρηνσ −

1

2
ηµνηρσ

)
σρσ(q) , (3.33)

is the standard saturated graviton propagator,

Πmassive =
1

2

∫
d4q

(2π)4
Jµν(−q) 1

q2 +m2
P (2+,m2)µν

ρσJρσ(q) , (3.34)

is the standard saturated propagator of a massive spin-two particle and the rest
is an expression that does not contain any pole in q. In (3.34), the mass of the
canonically normalized field is m2 = 2mTT

1 /bTT
4 , the source for the massive spin-two

is related to the source of torsion by

Jµν =
1√

−2mTT
1

∇ρτ
ρµν , (3.35)
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and

P (2+,m2)µν
ρσ = T (m2)(µ

(ρT (m2)ν)
σ) − 1

3
T (m2)µνT (m2)ρσ , (3.36)

with

Tµν
(
m2
)

= ηµν +
qµqν
m2

, (3.37)

is the usual transverse-traceless projector, put on shell.

Propagating graviton and massive 2−

It has already been discussed in [1] how to choose the coefficients of a completely
general MAG in such a way that only the graviton and a massive 2− propagate.
Here we show how to arrive at such a model in the restricted context of a hook-
antisymmetric MAG.

The conditions that remove all unwanted propagation are solved by

mTT
3 =

−24
(
bTT
1

)2
+ 16bTT

1 bTT
8 − 3

(
bTT
8

)2
4(bTT

1 )2
mTT

1 ,

bTT
3 =

−8
(
bTT
1

)2
+ 4bTT

1 bTT
8 −

(
bTT
8

)2
4bTT

1

, bTT
4 = bTT

7 = −2bTT
1 , bTT

9 = −bTT
3 .

(3.38)

With these parameters, the coefficient matrix for the 2− state becomes simply

b(2−) = −bTT
1 q2 −mTT

1 , (3.39)

and, since the projector P (2−) is of type TTT , the ghost- and tachyon-free conditions
are

mTT
1 > 0, bTT

1 > 0. (3.40)

This agrees with the result of [1]. Proceeding as in the previous section we can
recast the saturated propagator in the form (3.32), where now

Πmassive =
1

2

∫
d4q

(2π)4
Jλµν(−q) 1

q2 +m2
P (2−,m2)λµντρσJ

τρσ(q) , (3.41)

where m2 = mTT
1 /bTT

1 and P (2−,m2) is the 2− projector put on shell and

Jµνρ =
1√
bTT
1

τµνρ . (3.42)
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Propagating graviton and massive 1+

In order for the 2+ and 2− components not to propagate we must have bTT
1 = bTT

4 = 0,
and then for 1+ to propagate we must have bTT

7 ̸= 0. The remaining conditions
coming from the 1− and 0+ sectors imply for the other parameters:

mTT
3 = − mTT

1

4 (bTT
7 )

2

[
4
(
bTT
7

)2
+ 4bTT

7 bTT
8 + 3

(
bTT
8

)2]
, bTT

3 = −bTT
9 =

(
bTT
8

)2
4bTT

7

.

(3.43)

Then the kinetic coefficient is

b(1+) =
1

3

(
−bTT

7 q2 − 3mTT
1

)
. (3.44)

Taking into account that P (1+) contains a single longitudinal projector, the ghost-
and tachyon-free conditions are

mTT
1 < 0 , bTT

7 < 0 . (3.45)

The saturated propagator is again of the form (3.32), where now

Πmassive =
1

2

∫
d4q

(2π)4
Jµν(−q) 1

q2 +m2
P (1+,m2)µνρσJ

ρσ(q) , (3.46)

where the mass of the canonically normalized field is m2 = 3mTT
1 /bTT

7 and its source
(an antisymmetric two-tensor) is related to the torsion source by

Jµν =
1√

−6mTT
1

∇ρ(τ
ρ[µν] + τµρν) , (3.47)

and the projector is

P (1+,m2)µνρσ = T [µ
[ρ(m

2)T ν]
σ](m

2) = δ[ρ[µδ
σ]

ν] + 2
δ[ρ[µqν]q

σ]

m2
. (3.48)

Propagating graviton and massive 1−

In order to stop the propagation of 2+, 2−, 1+ and 0−, the coefficients must satisfy
the first four of the following conditions:

bTT
1 = bTT

4 = bTT
7 = 0 , bTT

9 = −bTT
3 , bTT

8 = 0 . (3.49)

In order to have only one propagating 1−, we must set to zero the coefficient of q4

in det[b(1−)], and this implies the last condition. There are two 1− representations
in the three-index tensor and their coefficient matrix is now

b(1−) =

(
−mTT

1 −mTT
3 − bTT

3 q2 − 1√
2

(
mTT

3 + bTT
3 q2

)
− 1√

2

(
mTT

3 + bTT
3 q2

)
1
2

(
−2mTT

1 −mTT
3 − bTT

3 q2
)) , (3.50)

49



This matrix has eigenvectors: (−1/
√

2, 1)T with eigenvalue −mTT
1 , and (

√
2, 1)T

with eigenvalue

1

2

(
−3bTT

3 q2 − 2mTT
1 − 3mTT

3

)
. (3.51)

It is the latter combination of states that propagates. Since the projectors P (1−)33
and P (1−)66 have zero and two longitudinal indices, respectively, there are no addi-
tional signs and the conditions for ghost- and tachyon-freedom are

bTT
3 > 0 , 2mTT

1 + 3mTT
3 > 0 . (3.52)

The saturated propagator for the massive state is

Πmassive =
1

2

∫
d4q

(2π)4
Jµ(−q) 1

q2 +m2
T (m2)µνJ

ν(q) , (3.53)

where the mass of the canonically normalized field is m2 = (2mTT
1 + 3mTT

3 )/3bTT
3

and its source (a vector) is related to the torsion source by

Jµ =
1

3
√
bTT
3

τµρρ . (3.54)

Propagating graviton and massive 0+

Let us finally focus on the 0+ state. By taking

bTT
1 = bTT

3 = bTT
4 = bTT

7 = bTT
8 = 0 , (3.55)

all modes except for 0+ become non-dynamical. Then, its kinetic coefficient is

a(0+)33 = −1

2
(3bTT

9 q2 + 2mTT
1 + 3mTT

3 ) . (3.56)

The projector P (0+)33 has one longitudinal index, so there is an additional minus
sign. Thus the conditions for ghost- and tachyon-freedom are

bTT
9 < 0 , 2mTT

1 + 3mTT
3 < 0 . (3.57)

The saturated propagator of the massive scalar is

Πmassive =
1

2

∫
d4q

(2π)4
J(−q) 1

q2 +m2
J(q) , (3.58)

where m2 =
(
2mTT

1 + 3mTT
3

)
/3bTT

9 and the source is

J =
1√

−3(2mTT
1 + 3mTT

3 )
∇µτλ

λµ . (3.59)
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Checking the result: vector torsion

Let us consider the special case of vector torsion:

Tµνρ = vµgνρ − vρgµν . (3.60)

Note that in this case the totally antisymmetric part is zero, so vector torsion is
automatically hook-antisymmetric. If we impose this condition as a kinematical
constraint, and also enforce the restrictions (3.21) on the coefficients, the Lagrangian
becomes

LE = −9

2
bTT
3 ∇µvν∇µvν − 9

2
bTT
9 (∇µv

µ)2 − 3

2

(
2mTT

1 + 3mTT
3

)
vµv

µ . (3.61)

We can then distinguish the two subcases when v is transverse or longitudinal.
Imposing ∇µv

µ = 0, v has spin/parity 1− corresponding to the transverse mode.
Then, imposing the conditions (3.49) so that only 1− propagates, the linearized
Lagrangian becomes

LE = vµη
µν

[
−9

2
bTT
3 q2 − 3

2

(
2mTT

1 + 3mTT
3

)]
vν . (3.62)

So this confirms the ghost- and tachyon-free conditions (3.52). Imposing that vµ =
∇µψ, with ψ a 0+ field (a true scalar) and imposing the conditions on the coefficients
for the propagation of 0+ only, the linearized Lagrangian becomes

LE = −9

2
bTT
9 ψ22ψ +

9

2

(
2mTT

1 + 3mTT
3

)
ψ2ψ . (3.63)

This has the same form as (3.16) and, treating it in the same way, we find that the
only propagating degree of freedom has linearized Lagrangian

LE =
3

2

2mTT
1 + 3mTT

3

bTT
9

ψ2 (3bTT
9 q2 + 2mTT

1 + 3mTT
3 )ψ2 . (3.64)

This confirms the conditions (3.57).

3.3 From hook-antisymmetric MAGs to hook-symmetric

MAGs

In [49] the same procedure that we have followed for constructing simple hook-
antisymmetric MAGs has been used to obtain simple hook-symmetric MAGs. We
will now show that it is possible to obtain these simple hook-symmetric models
starting from our hook-antisymmetric ones using a simple trick. Since the spaces
of hook-symmetric and hook-antisymmetric tensors have the same dimension, it
is possible to construct an isomorphism between the two. In particular, given a
hook-symmetric (in the last two indeces) tensor Qabc, is possible to build a hook-
antisymmetric (in the first and third indeces) tensor via the very simple relation:

T abc = Qabc −Qcba . (3.65)
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Note that hook-symmetric tensors and hook-antisymmetric ones have the same
spin-parity content. Inserting (3.65) in (3.22) and using the fact that for a hook-
symmetric tensor

MQQ
2 = −1

2
MQQ

1 , MQQ
4 =

1

4
MQQ

3 , MQQ
5 = −1

2
MQQ, (3.66)

HQQ
2 = −1

2
HQQ

1 , HQQ
4 = 4HQQ

3 , HQQ
5 = −2HQQ

3 (3.67)

HQQ
8 = −HQQ

7 +
1

2
HQQ

6 , HQQ
9 = −1

2
HQQ

6 , HQQ
11 = −2HQQ

10 (3.68)

HQQ
12 = −2HQQ

10 , HQQ
13 = 4HQQ

10 , HQQ
15 =

1

4
HQQ

14 (3.69)

HQQ
16 = −1

2
HQQ

14 , HRQ
5 = −1

2
HRQ

4 , HRQ
7 = −1

2
HRQ

6 .

(3.71)

we arrive at the most general hook-symmetric Lagrangian

LE = −1

2
mQQ

1 MQQ
1 − 1

2
mQQ

3 MQQ
3 − 1

2
bQQ
1 HQQ

1 − 1

2
bQQ
3 HQQ

3 − 1

2
bQQ
6 HQQ

6

−1

2
bQQ
7 HQQ

7 − 1

2
bQQ
10 H

QQ
10 − 1

2
bQQ
14 H

QQ
14 − 1

2
bRQ
4 HRT

3 − 1

2
bRQ
6 HRT

3 . (3.72)

with the new couplings bQQ related to the old couplings bTT via

mTT
1 = −1

6
mQQ

1 (3.73a)

mTT
3 = −2

9
mQQ

3 (3.73b)

bTT
1 =

1

3
bQQ
1 (3.73c)

bTT
3 =

1

9
bQQ
3 (3.73d)

bTT
4 =

4

9
bQQ
6 +

1

9
bQQ
7 (3.73e)

bTT
7 = −2

9
bQQ
6 +

4

9
bQQ
7 (3.73f)

bTT
8 =

1

9
bQQ
10 (3.73g)

bTT
9 =

4

9
bQQ
14 (3.73h)

bRT
3 =

3

2
bRQ
4 (3.73i)

bRT
5 =

3

2
bRQ
6 (3.73j)

Using these transformation laws it is possible to translate the constraints on the
couplings bTT in constraints on the couplings bQQ. For example, let us consider the
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case of the propagating spin-2− particle. The conditions (3.38) become, after some
trivial algebra,

mQQ
3 =

−72
(
bQQ
1

)2
+ 16bQQ

1 bQQ
10 −

(
bQQ
10

)2
16
(
bQQ
1

)2 mQQ
1 ,

bQQ
3 =

−72
(
bQQ
1

)2
+ 12bQQ

1 bQQ
10 −

(
bQQ
10

)2
12bQQ

1

, bQQ
6 =

1

2
bQQ
7 = −bQQ

1 , bQQ
14 = −1

4
bQQ
3 .

(3.75)

These are in agreement with the results of [49]. The conditions (3.40) becomes

mQQ
1 > 0, bQQ

1 > 0, (3.76)

also in agreement with [49]. Similarly, it is possible to recover the other models
proposed in [49] applying the above mapping between the couplings of the hook-
symmetric and hook-antisymmetric theories.

3.4 General antisymmetric MAGs

In order to simplify the discussion, in the preceding sections we have assumed that
torsion is either totally antisymmetric or hook-antisymmetric. These kinematical
restrictions have the effect of reducing the number of independent terms in the La-
grangian, so the identification of viable models with the desired properties becomes
algebraically simpler. One may ask whether simple MAGs with a single healthy
propagating degree of freedom, in addition to the graviton, exist also in the context
of general antisymmetric MAGs. A priori the answer is not obvious, because we are
now working in a larger space of theories (where in principle more solutions could
exist) but we also have more equations, because there are more degrees of freedom
whose propagation we want to inhibit. It turns out that the first effect prevails, and
there are several more solutions than in the kinematically restricted cases. These
solutions have different b- and m-coefficients and correspondingly different masses.
The reader can derive these models by imposing conditions on the general kinetic
coefficients given in Appendix B, and following the general procedure outlined in
the previous sections. We will not try to systematically list all these cases.

3.5 Discussion

The most famous antisymmetric MAGs are PGTs, which have a Lagrangian quadratic
in curvature and torsion. There are only few of them without ghosts and tachyons
and without accidental symmetries [15,16]. We have seen that when we allow general
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dimension-four terms in the Lagrangian, the number of solutions increases consid-
erably. In this Chapter we have only considered “simple” MAGs, in the sense that
only one degree of freedom propagates in addition to the graviton, and we found
that there are solutions for every possible choice of the additional degree of free-
dom. The cases we have considered are such that all the non-propagating degrees
of freedom have mass terms and therefore must vanish on shell. One could also
consider cases when these masses go to zero, but then one would have to make sure
that the gauge invariances arising in this way extend to the nonlinear theory. One
can generalize our construction to cases with two, three or possibly more healthy
propagating degrees of freedom, and a full classification seems daunting. An analy-
sis similar to the one of this Chapter as been performed for symmetric MAGs, i.e.
theories without torsion but with nonmetric connection [49] and we have shown how
it is possible to recover these results using an isomorphism between hook-symmetric
and hook-antisymmetric tensors.

One interesting phenomenon that can present itself is that the good propagation
of one degree of freedom implies some pathology for another. The simplest example
of this is the theory of a vector field. Normally we choose the Lagrangian of a
vector field to be of Proca form, because we require that only spin-1 propagates,
but suppose we want also spin-0 to propagate. We can achieve this by adding to the
Lagrangian a term of the form ∇µA

µ. But it is well known that such a theory has
pathologies. In fact we saw in section 3.1 that the mass has necessarily a wrong sign
either for 1− or for 0+. One can trace this problem to the fact the 1− is transverse
and 0+ is longitudinal. We have seen that the phenomenon occurs also for vector
torsion and for axial vector torsion, for a similar reason. In fact, we can say that in
general such problems will arise when a given parameter affects the propagation of
degrees of freedom with different numbers of longitudinal and transverse indices.

We have presented our examples of simple MAGs in the Einstein form, i.e. treat-
ing torsion as an independent field and writing the Lagrangian in terms of the Rie-
mannian curvature and covariant derivative. In this form MAG looks like a metric
theory of gravity coupled to a peculiar form of matter. The alternative Cartan form
of MAG, where the Lagrangian is written in terms of the curvature and covariant
derivative constructed from the independent connection, offers an equivalent de-
scription that may be preferable from some points of view. While the models we
have presented look somewhat trivial in the Einstein form, in the sense that they
are “just” GR coupled to some scalar, vector or tensor matter, this “simplicity” of
the models is much less obvious in the Cartan form, where Yang-Mills-like terms are
present in addition to the Palatini one. In view of possible applications of MAG to
the dark matter (or dark energy) problems it is amusing to observe that the equiv-
alence between the two formulations of MAG suggests that the dichotomy between
modifying gravity and adding dark matter may be more a semantic issue than a real
physical one.
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Chapter 4

On shell all matter-s in the
cosmological constant problem

4.1 Introduction

The cosmological constant problem is probably one of the most important open
issues in theoretical physics. A common way of presenting this problem proceeds
along the following lines (see e.g. [50]). Let us consider a quantum field in Minkowski
space. Because of Lorentz invariance, the vacuum expectation value (VEV) of its
the Energy-Momentum (EM) tensor should have the form 1

⟨Tµν⟩vac = −⟨ρ⟩vac gµν , (4.1)

Naively, one can think of the field as an infinite collection of oscillators, hence the
vacuum energy density is the sum of the vacuum energies of all the oscillators. In
flat space, putting a cutoff C on the spatial momenta, 2 one gets

⟨ρ⟩vac =

∫ C

0

d3q

(2π)3
1

2

√
q2 +m2

= 4π
1

(2π)3
1

2

∫ C

0

dqq2
√
q2 +m2

=
1

(4π)2

[
C(C2 +m2)3/2 − 1

2
m2C

√
m2 + C2 − 1

2
m4 log

(
C +

√
m2 + C2

m

)]

=
1

(4π)2

[
C4 +m2C2 − 1

2
m4 log

(
2C

m

)
+
m4

8

]
+O(1/C2) . (4.2)

This expression has quartic, quadratic and logarithmic divergences. The same con-
clusion can be reached in a more formal way by calculating the Euclidean effective
action. Since a curved manifold looks like flat spacetime at short distances, the di-
vergences of a quantum field in curved spacetime are the same as in flat spacetime.

1Here we work in signature − + ++, but the rest of the Chapter is based on Euclidean calcu-
lations.

2We reserve the symbol Λ for the cosmological constant.
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Because of this reason, is usually assumed that the flat space calculation gives the
correct Energy-Momentum tensor to be used in the semiclassical Einstein equations

Rµν −
1

2
Rgµν + Λgµν = 8πG⟨Tµν⟩ . (4.3)

This results in a diverging curvature. It seems that the first person to come up with
this argument was Pauli (unpublished, see [51]). He assumed what we would likely
consider a very small cutoff C of the order of the mass of the electron, and discovered
that the universe should not extend further than the Moon. Nowadays the problem
has become even worse [52], since we know that quantum field theory is valid way
beyond the scale of the electron. This appears to be the greatest discrepancy ever
discovered between theory and observations.

A simple way out is to assume that a “bare” cosmological term cancels most or
all of the vacuum energy, but in this way we are just trading a problem with another
since we should now uncover a mechanism able to explain a terrific amount of fine
tuning. 3

While intuitive, the computation by Pauli has been criticized as being too naive
by several authors [53–56] 4. An important critic raised firstly by Akhmedov [53], and
then by Ossola and Sirlin [54], was that the momentum cutoff breaks the Lorentz
invariance that was assumed in (4.1). This can be seen as follows. The energy-
momentum tensor is an integral over the Lorentz invariant phase space

⟨T µν⟩vac =
1

(2π)3

∫
d3q

2ω(q)
qµqν (4.4)

where ω(q) =
√
m2 + q2 of which (4.5) is the 00 component. Assuming only rota-

tional invariance, we can choose coordinates such that q0q0 = ω(q)2, q0qi = 0 and
qiqj = 1

3
q2δij, and since ⟨T ij⟩vac = pδij we find

⟨p⟩vac =
1

(2π)3

∫
d3q

2ω(q)

q2

3

=
1

(4π)2

[
C(C2 +m2)3/2

3
− 5

6
m2C

√
m2 + C2 +

1

2
m4 log

(
C +

√
m2 + C2

m

)]

=
1

(4π)2

[
C4

3
− m2C2

3
+

1

2
m4 log

(
2C

m

)
− 7m4

24

]
+O(1/C2) , (4.5)

that is not equal to −⟨ρ⟩vac.
By considering alternative regularization methods that preserve Lorentz invari-

ance, these authors concluded that the vacuum energy of free quantum fields cannot
diverge more than quadratically. This is significant, but not enough to solve the

3Another possible solution is offered by unimodular gravity, in which the total volume of space-
time is not dynamical. Having fixed the total volume, it is natural to further fix the whole volume
form by a gauge choice. This solves the issue of the cosmological constant, but it is hard to imagine
how to test unimodular vs. ordinary gravity. In the following we will assume that the total volume
is dynamical and focus on the calculation of the vacuum energy.

4see also [57]

56



problem, and in any case interacting fields could still give rise to a quartic diver-
gence.

Pauli went further by noticing that there can be cancellations between the con-
tributions of bosons and fermions. What matters for the real world is not the
contribution of a single field but rather the sum of all the contributions of all fields.
Thus for the energy density one would consider

⟨ρ⟩vac =
∑
n

(−1)2sngn
1

(4π)2

[
C4 +m2

nC
2 − 1

2
m4

n log

(
2C

mn

)
+
m4

n

8

]
+O(1/C2) .(4.6)

where sn is the spin of the n-th particle species, mn its mass and gn = 2sn + 1 is
the multiplicity factor due to spin (in this way we must count separately different
flavors, colors etc.). Similarly for the pressure one has

⟨p⟩vac =
∑
n

(−1)2sngn
1

(4π)2

[
C4

3
− m2

nC
2

3
+

1

2
m4

n log

(
2C

mn

)
− 7m4

n

24

]
+O(1/C2) .(4.7)

Splitting log 2C
mn

= log 2C
µ
− log mn

µ
, where µ is an arbitrary scale, we see that in

order to avoid divergences in ⟨ρ⟩vac in the limit C → ∞, one would have to demand∑
n

(−1)2sngn = 0 , (4.8)∑
n

(−1)2sngnm
2
n = 0 , (4.9)∑

n

(−1)2sngnm
4
n = 0 , (4.10)

These conditions strongly restrict the particle spectrum. It has been observed in [58]
that finiteness of the energy-momentum tensor is equivalent to Lorentz invariance.
Indeed, Lorentz invariance means that ⟨p⟩vac = −⟨ρ⟩vac. Comparing (4.6) and (4.7),
we see that this implies the three Pauli sum rules (4.8),(4.9),(4.10). But then the
energy density and pressure are finite and equal to:

⟨ρ⟩vac = −⟨p⟩vac =
1

64π2

∑
n

(−1)2sngnm
4
n log

(
m2

n

µ2

)
. (4.11)

Note that, because of (4.10), this expression is independent of µ. Conversely, finite-
ness of ⟨ρ⟩vac implies that the first three conditions, polynomial in the masses, must
be satisfied, and then the remaining terms satisfy the condition for Lorentz invari-
ance.

An interesting twist has been added to this line of thought very recently in the pa-
per [59]. The authors randomly generate mass spectra and measure ⟨ρ⟩vac for a fixed
cutoff C. The resulting distribution is Gaussian, centered at zero. In a separate run,
the mass spectra are restricted so as to satisfy the condition of Lorentz invariance.
In this case the distribution is again Gaussian, centered at zero, but much narrower.
The standard deviation of the distribution can be taken as an estimate for the typical
value of ⟨ρ⟩vac. In the Lorentz invariant case, it is found that it changes logarithmi-
cally with the cutoff. Thus one finds that, if the particle spectrum was a random
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variable, but constrained by the condition of Lorentz invariance, the probability of
finding a vacuum energy that is much greater than logC/µ is exponentially small.

* * *
A new way of addressing the problem has been recently proposed by Becker and

Reuter. Coming back to the usual procedure of computing the Energy-Momentum
tensor in flat background and then to insert it in the Einstein equations, they have
argued that this way of preceeding is inconsistent because one uses the EM tensor
computed in one metric as the source of another metric: the metric has a nontrivial
effect on the expectation value of the EM tensor that cannot be ignored and changes
the result drastically. What they argue is that one has to calculate the EM tensor
self-consistently, in the metric that solves the semiclassical Einstein equations (4.3)
in the presence of that EM tensor [60, 61]. This is, in general, a very hard task.
Since the problem of the cosmological constant concerns only the overall scale of
the universe, as a first step, one can consider a one-parameter family of geometries
characterized by a single scale. Becker and Reuter have considered a maximally
symmetric background, where the only free parameter of the metric is the radius, or
equivalently the scalar curvature R. The concrete calculation (that we shall review
in Section 4.2) is done for a quantum scalar field in Euclidean space, i.e. on a
sphere. Since the spectrum of the kinetic operator is discrete, it is natural to put a
cutoff N on the principal quantum number when computing the Effective Action.
For fixed N , one can then compute the curvature self-consistently and surprisingly it
decreases like 1/N2. This result has been extended also to the noncompact, negative
curvature case [62].

4.2 Quantum fields on Euclidean De Sitter space

In this section we review the general logic of the calculation of [60], following the
treatment in [63]. We assume that we are in a semiclassical regime where the metric
gµν can be treated as a classical field with the (Euclidean) Einstein-Hilbert action
(and cosmological term)

SH(g) =
1

16πG

∫
d4x

√
g [2Λ −R] , (4.12)

interacting with a quantum field ϕ with action Sm(ϕ; g). The backreaction of the
quantum field is encoded in the one loop effective action (EA). Even though the
reader could be familiar with this object, we will present here its derivation, in
particular to underline the role played by the functional measure. For the time being
we will consider the case of a free scalar field and refer to the induced gravitational
effective action as Γ[g], even though later we will use the symbol Γ to indicate the
total effective action, comprising also the classical Einstein-Hilbert term and the
classical action of matter. After this premise, we can start our computation from
the very definition of Γ[g]:

e−Γ[g] =

∫
D(ϕ, g)e−Sm(ϕ,g) . (4.13)
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The measure we are assuming is the Fujikawa one [64–66], given by

D(ϕ, g) =
∏
x

[detgµν(x))]
1
4dϕ(x)/µ , (4.14)

where µ is an arbitrary scale introduced to make the measure dimensionless. It is
assumed that the path integral has been regularized restricting it to only a finite
number of spacetime points, and to each point x it is attached an integration variable
ϕ(x). Let ∆ = −∇2 +E be the kinetic operator of the scalar field and let us assume
that we know the eigenfucntions χn,m and the (possibly degenerate) eigenvalues λn
of this operator, i.e. we have solved the eigenvalue problem

∆χn,m(x) = λnχn,m(x) . (4.15)

Being ∆ a self-adjoint operator, the χn,m form a complete orthogonal basis for the
functions defined on the Euclidean spacetime manifold M, that we assume compact
and without boundary. We will further assume that these functions have been
orthonormalized with respect to the inner product of L2(M), so that

µ2

∫
d4x

√
gχ∗

n,m(x)χp,q(x) = δn,pδm,q (4.16)

µ2
∑
n,m

χn,m(x)χ∗
n,m(y) =

δ(x− y)
√
g

(4.17)

To compute the functional integral, the first step is to introduce the new integration
variable

φ(x) = g
1
4 (x)ϕ(x) (4.18)

which transforms as a scalar density. In this way the transformed measure becomes
metric independent:∫ ∏

x

g
1
4 (x)dϕ(x)e−

1
2

∫
d4x

√
gϕ∆ϕ =

∫ ∏
x

dφ(x)e−
1
2

∫
d4xφ∆̃φ , (4.19)

where

∆̃ = g
1
4 (x)∆g−

1
4 (x) (4.20)

The eigenfunctions of this new operator are simply given by

ζn,m(x) = g
1
4 (x)χn,m(x) , (4.21)

while the eigenvalues are the same as the ones of ∆:

∆̃ζn,m(x) = λnζn,m(x) . (4.22)

The functions ζn,m(x) satisfy the completeness and orthonormality conditions

µ2

∫
d4x ζ∗n,m(x)ζp,q(x) = δn,pδm,q (4.23)

µ2
∑
n,m

ζn,m(x)ζ∗n,m(y) = δ(x− y) . (4.24)
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We can now easily compute the functional integral. The first step is to expand the
field φ(x) in the basis of the ζn,m(x):

φ(x) =
∑
n,m

βn,mζn,m(x) . (4.25)

Next we change variables from the φ(x) to βn,m. The Jacobian is

Jn,m(x) =
∂φ(x)

∂βn,m
= ζn,m (4.26)

Being the ζn,m(x) orthonormal this matrix is orthogonal with unit determinant (up
to irrelevant µ factors). Hence, we have just to compute the trivial Gaussian integrals∏

n,m

∫
dβn,me

− 1
2

∑
n,m

λn
µ2

β2
n,m . (4.27)

Hence

e−Γ[g] =

(∏
n,m

λn
µ2

)− 1
2

. (4.28)

In the end

Γ[g] =
1

2

∑
n,m

log

(
λn
µ2

)
≡ 1

2
Tr log

(
∆

µ2

)
. (4.29)

The total effective action will be the sum of this one loop contribution with the
classical action of the scalar and the Einstein-Hilbert action, hence:

Γ(g, ϕ) = SH(g) + Sm(g, ϕ) +
1

2
Tr log

(
∆/µ2

)
(4.30)

Variation of the EA with respect to the metric yields the semiclassical Einstein
equations5

Rµν −
1

2
Rgµν + Λgµν = 8πG⟨Tµν⟩ (4.31)

where the l.h.s. comes from the classical Einstein-Hilbert action (with a bare cosmo-
logical term) and the r.h.s is the VEV of the EM tensor of the quantum field. The
derivation of the effective action for spinors, vector fields and metric fluctuations
proceed along similar lines, see for example [61].

For our purposes it will be enough to study the EA on a Euclidean De Sitter
space, i.e. a sphere S4. Then, the only metric degree of freedom is the radius ℓ, or

5Obviously, the variation of the effective action with respect to the scalar field gives the equation
of motion of the latter. Since we are considering a free field, this equation is simply the Klein-
Gordon equation, possibly with a non-minimal coupling term. The solution of this equation is
trivially ϕ = 0.
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equivalently the (constant) scalar curvature R = 12/ℓ2. The equations (4.31) reduce
to the single trace equation

−R + Λ = 8πG⟨T µ
µ ⟩ . (4.32)

We can also obtain this equation directly by deriving the EA with respect to R. For
example, at classical level, recalling that the volume of the four-sphere is

V4 =
384π2

R2
, (4.33)

the Einstein-Hilbert action for a spherical metric can be written

SH(R) =
48πΛ

GR2
− 24π

GR
(4.34)

and deriving with respect to R we obtain the classical equation

R = 4Λ . (4.35)

Aside from eliminating all gravitational degrees of freedom, except for the overall
scale, the advantage of working on a sphere is that the spectrum of Laplacians is
well-known and therefore it is possible to calculate the EA without resorting to heat
kernel asymptotics.

The operation Tr in the definition (4.29) of the EA is a functional trace that has
to be regulated. We regulate the sum by putting an upper bound N on the principal
quantum number ℓ:

1

2
TrN log

(
∆/µ2

)
=

1

2

N∑
ℓ=1

mℓ log
(
λℓ/µ

2
)
, (4.36)

We can compare this procedure to the more standard one of cutting off the sum at
some cutoff C with dimension of mass, such that

λℓ < C2 . (4.37)

At this stage there is no significant difference between the two procedures, because
the dimensionless and the dimensionful cutoffs are simply related by

C2 = λN . (4.38)

In fact, the divergences for N → ∞ match those for C → ∞. However, we shall see
in the following that when we demand that the background metric satisfies Einstein’s
equations, the two procedures lead to very different conclusions.

In the next sections we specify the calculation to fields with different spins: we
consider scalar fields, fermions, vector fields and the graviton.
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4.3 Scalar field

For a scalar field, the eigenvalues and their multiplicities are

λℓ =
R

12
ℓ(ℓ+ 3) + E , mℓ =

1

6
(ℓ+ 1)(ℓ+ 2)(2ℓ+ 3) (4.39)

where E is the squared mass plus possibly a nonminimal term proportional to R,
and ℓ = 0, 1 . . . . In the massless, minimally coupled case, the EA is

ΓN(R) =
48πΛ

GR2
− 24π

GR
+

1

2
fS(N) log

(
R

12µ2

)
+

1

2
TS(N, 0) , (4.40)

where

fS(N) =
N∑
ℓ=1

mℓ =
1

12
N(N + 4)(N2 + 4N + 7) (4.41)

is the total number of scalar modes included in the trace and

TS(N, z) =
N∑
ℓ=1

mℓ log (ℓ(ℓ+ 3) + z) , (4.42)

is the quantum trace for a sphere of radius R = 12µ2 and z = 12E/R. The functions
fS and TS diverge quartically for N → ∞, In the following we shall also need the
function

SS(N, z) ≡ ∂TS(N, z)

∂z
=

N∑
ℓ=1

mℓ
1

ℓ(ℓ+ 3) + z
(4.43)

that only diverges quadratically.
The equation of motion for the metric is 6

24π

GR3
(−R + 4Λ) =

1

2R
fS(N) , (4.44)

whose solution is a sphere of curvature

R =
24π

GfS(N)

(
−1 ±

√
1 +

GΛfS(N)

3π

)

= 48

√
πΛ

G

(
1

N2
− 4

N3

)
+

(
600

√
πΛ√
G

− 288π

G

)
1

N4
+ . . . (4.45)

where in the expansion we have selected the solution with the upper sign, because
the other gives negative curvature. This is Becker and Reuter’s main result. We
see that, opposite to standard lore, the curvature of spacetime decreases in units of√

Λ/G, when more quantum modes are included in the calculation.

6This is just the trace of (4.3).
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In the massive case, the EA for the metric becomes

ΓN(R) =
48πΛ

GR2
− 24π

GR
+

1

2
fS(N) log

(
R

12µ2

)
+

1

2
TS

(
N,

12m2

R

)
. (4.46)

The quantum trace is independent of ϕ, so the scalar potential does not receive any
quantum corrections. Since the sum is finite, we can take the derivative under the
sum, so that the equation of motion for the metric can be written in the form

24π

GR3
(−R + 4Λ) =

1

2R

[
fS(N) − 12m2

R
SS

(
N,

12m2

R

)]
. (4.47)

This equation cannot be solved analytically, but one can make an ansatz

R =
K2

N2
+
K3

N3
+
K4

N4
+ . . . (4.48)

and determine the coefficients Kn iteratively. Expanding for small masses (and
assuming Λ > 0)

K2 = 48

√
πΛ

G
+ 12m2 +O(m4) (4.49)

K3 = −192

√
πΛ

G
− 48m2 +O(m4) (4.50)

K4 =

(
600

√
πΛ√
G

− 288π

G

)
+ 128m2 + . . . (4.51)

A few comments on orders of magnitude are in order: in these calculations it
seems natural to choose Λ of order one in Planck units. Then the coefficient K2 is of
the order of the square Planck mass. If we were to choose Λ = 0, there would still be
a N−2 suppression with a much smaller coefficient K2, of the order of the square of
the scalar mass. If Λ = 0 and the scalar field is also massless, the solution with the
upper sign in (4.45) is identically zero. The one with the lower sign has K2 = 0 and
K3 = 0, and R decreases like N−4, with a coefficient K4 that is again of order one in
Planck units, but negative, so not compatible with the assumed positive curvature.
This problem is specific to the scalar field and we shall return to it later when we
discuss other matter fields.

4.4 Fermion

We consider now the case of a massless Dirac field minimally coupled to gravity.
The effective action of the system is

ΓN(g, ψ) = SH(g) + Sm(g, ψ) − TrN log(D/µ) (4.52)

where D is the Dirac operator. Its eigenvalues and multiplicities are given by [67]

λ±ℓ = ±
√
R

12
(ℓ+ 2) , mℓ = 4

(
ℓ+ 3

ℓ

)
, ℓ = 0, 1, 2 . . . (4.53)
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The trace sum is over the eigenvalues with ℓ ≤ N . We follow the standard method
of evaluating TrN log(D/µ) = 1

2
Tr log(D2/µ2) [68].

On a spherical background, the effective action (4.52) becomes

ΓN(R) =
48πΛ

GR2
− 24π

GR
− 1

2
fD(N) logR/µ2 + C(N) , (4.54)

where

fD(N) = 2
N∑
ℓ=0

mℓ =
1

2
(N + 1)(N + 2)(N + 3)(N + 4) (4.55)

=
1

3
(N4 + 10N3 + 35N2 + 50N + 24) (4.56)

is the total number of modes with ℓ < N (the factor two is due to the existence of
eigenvalues with both signs). The coefficient of the N4 term is four times that of fS,
reflecting that a Dirac spinor has four degrees of freedom. Furthermore, extremizing
the action with respect to R, amounts to solving

24π

GR3
(−R + 4Λ) = − 1

2R
fD . (4.57)

The solutions of this equation are

R =
24π

GfD

[
1 ±

√
1 − GΛfD

3π

]
(4.58)

In order for the solution to be real we must have GΛfD
3π

< 1. If Λ > 0, this only
happens for a finite range of values of N . For negative Λ the solutions exist for all
N , and the one with the upper sign goes like

R = 24

√
π|Λ|
G

1

N2
+O

(
1

N3

)
(4.59)

Remarkably, this is the same solution that we found for the scalar, aside from a
factor 2.

Let us now generalize to the case of a fermion with mass mD. In this case the
effective action reads

ΓN =
48πΛ

GR2
− 24π

GR
− 1

2
fD(N) log

(
R

12µ2

)
− 1

2
TD(N, zD) , (4.60)

where from (4.42) we have introduced the function

TD(N, z) = 2
N∑

n=0

mn log ((2 + n)2 + z) (4.61)

with the parameter z = zD

zD =
12m2

D

R
. (4.62)
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The equation of motion is analogous to (4.47) and is given by:

24π

GR3
(−R + 4Λ) =

1

2R
(−fD + zDSD(N, zD)) , (4.63)

with the function SD defined from (4.43), namely

SD(N, z) =
∂TD(N, zD)

∂z
= 2

N∑
ℓ=0

mℓ
1

(2 + ℓ)2 + zD
. (4.64)

We can search solutions with the form

R =
K2

N2
+
K3

N3
+
K4

N4
+ . . . (4.65)

Inserting into the equation of motion and asking for the divergences N6, N5 and N4

to cancel, we get the equation

K2
2 − 24K2m

2
D + 576πGΛ + 288m4

D log

(
1 +

K2

12m2
D

)
= 0 (4.66)

for K2, and similar ones for K3 and K4, which can be solved in the limit mD → 0.
Assuming Λ < 0 we obtain

K2 = 24

√
−πΛ

G
+ 12m2

D +O(m3
D) (4.67)

K3 = −120

√
−πΛ

G
− 60m2

D +O(m3
D) (4.68)

K4 = −480

√
−πΛ

G
+ 72

π

G
+ 12m2

D

[
127

6
+ 3

√
− π

GΛ
+ log

(
Gm2

D

2
√
−πGΛ

)]
+O(m3

D)(4.69)

As in the case of the scalar, if we choose Λ = 0 the mass of the fermion gives the
dimension to the coefficient K2. However, if the fermion is massless, K2 = 0 and
the first nonzero coefficient is K4, that this time is positive. Thus the choice Λ = 0
is possible for purely fermionic massless matter, but not for massless scalars. 7 We
shall return to this point later.

4.5 Maxwell field

Now we want to consider an abelian gauge field Aµ. To fix the gauge we have
to include in the matter action a gauge fixing term for the gauge boson and the
associated ghost contribution. The Euclidean gauge fixed action is

SM =

∫
d4x

√
g

[
1

4
FµνF

µν − 1

2α
(∇µA

µ)2 + ∇µc̄∇µc

]
, (4.70)

7One has to take the limit mD → 0 before the limit Λ → 0.
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where α is a gauge parameter. Commuting derivatives, the bosonic part of this
action is

1

2

∫
d4x

√
gAµ

[
−∇2gµν +

(
1 − 1

α

)
∇µ∇ν +

1

4
Rgµν

]
Aν . (4.71)

The standard way to get rid of the nonminimal terms ∇µ∇ν in the operator is to
choose the Feynman gauge α = 1. We can avoid fixing the gauge parameter by
decomposing Aµ in its transverse and longitudinal components

Aµ = aµ + ∇µϕ (4.72)

with

∇µa
µ = 0 . (4.73)

In this way the action becomes

S =

∫
d4x

√
g

[
1

2
aµ

(
−∇2 +

R

4

)
aµ +

1

α
ϕ(−∇2)2ϕ+ ∇µc̄∇µc

]
. (4.74)

The decomposition (4.72) is a change of variables that has a Jacobian J = det′(−∇2/µ2),
where the prime means that the zero mode has to be left out.

The effective action for the system is therefore given by

ΓN(g, a, ϕ, c̄, c) = SEH(g) + Sm(g, a, ϕ, c̄, c)

+
1

2
TraN log

((
−∇2 +

R

d

)
1

µ2

)
+

1

2
TrϕN log

(
(−∇2)2

1

µ4

)
− Trc̄cN log

(
(−∇2)

1

µ2

)
− 1

2
Tr′JN log

(
(−∇2)

1

µ2

)
. (4.75)

Importantly, the contributions of the longitudinal photon and of the ghosts cancel
exactly. For the transverse field the eigenvalues and multiplicities are

λℓ =
ℓ(ℓ+ 3) − 1

12
R , mℓ =

1

2
ℓ(ℓ+ 3)(2ℓ+ 3) . (4.76)

The Jacobian is a scalar determinant, so its calculation is based on the eigenvalues
and multiplicities given previously.

The effective action can then be expressed as

ΓN =
48πΛ

GR2
− 24π

GR
+

1

2
fM log

R

12µ2
+

1

2
Ta(N,−1) − 1

2
TS(N, 0) . (4.77)

Here the total number of physical degrees of freedom is

fM = fa − fS =
1

6
N(N3 + 8N2 + 17N + 4) , (4.78)

with fa and fS the total number of modes of the transverse vector and the Jacobian,
respectively. The function Ta is defined similarly to (4.42), but with the eigenvalues
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(4.76). We observe that the coefficients of the N4 and N3 terms are exactly twice
those of a scalar, reflecting the fact that a Maxwell field has two degrees of freedom.

Extremizing the effective action with respect to R yields

0 =
24π

GR3
(R− 4Λ) +

1

2R
fM . (4.79)

This is exactly the same equation of the scalar case, except for the replacement of
fS by fM . Again we have to choose the solution with the positive sign, and assume
Λ > 0, leading to

R ≈ 16

√
3πΛ

G

(
1

N2
− 4

N3

)
+

(
−232

√
3πΛ√
G

+
96π

G

)
1

N4
+ . . . (4.80)

We emphasize that the result is fully independent of the gauge parameter α. This is
due to the fact that the background Maxwell field Aµ = 0 is a solution of the equa-
tions of motion. Moreover, we observe that the coefficient K4 is positive, analogously
to the case of Dirac fields.

4.6 Graviton

Next we consider the case of metric fluctuations. Also in this case we need to include
a gauge fixing term and the corresponding ghost action. Furthermore, we choose to
use the exponential parametrization of the metric

gµν = ḡµρ(e
h)ρν , (4.81)

where h in the exponent is a mixed tensor hρν such that hµν = ḡµρh
ρ
ν is symmetric.

For the graviton field we use the York decomposition

hµν = hTT
µν + ∇̄µξν + ∇̄νξµ + ∇̄µ∇̄νσ − 1

4
ḡµν∇̄2σ +

1

4
ḡµνh , (4.82)

where hTT
µν is transverse and traceless, the vector ξ is transverse and all covariant

derivatives are calculated with the background metric. It is very convenient to
choose the “unimodular” gauge h = 0, that removes one of the three gauge degrees
of freedom. The remaining invariance under volume-preserving diffeomorphisms can
be fixed by the condition Fµ = 0, where

Fµ =

(
δνµ − ∇̄µ

1

∇̄2
∇̄ν

)
∇̄ρh

ρ
ν =

(
∇̄2 +

R

4

)
ξµ . (4.83)

As discussed in [69] (Section 5.4.6), this leads to a very simple form for the (off-shell)
effective action

Γ(ḡ) = S(ḡ) +
1

2
Tr log

(
∆(2)/µ

2
)
− 1

2
Tr log

(
∆(1)/µ

2
)
, (4.84)

where

∆(2) = −∇̄2 +
1

6
R̄ (4.85)
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acts on hTT
µν and

∆(1) = −∇̄2 − 1

4
R̄ (4.86)

acts on ξµ.
The spectra of these operators are

λ
(2)
ℓ =

ℓ(ℓ+ 3) − 2

12
R , m

(2)
ℓ =

5

6
(ℓ+ 4)(ℓ− 1)(2ℓ+ 3) (4.87)

with ℓ = 2, 3 . . . and

λ
(1)
ℓ =

ℓ(ℓ+ 3) − 6

12
R , m

(1)
ℓ =

1

2
ℓ(ℓ+ 3)(2ℓ+ 3) (4.88)

with ℓ = 2, 3 . . .
Altogether, the effective action can be expressed in terms of the T-functions and

the number of degrees of freedom

ΓN =
48πΛ

GR2
− 24π

GR
+

1

2
(f (2) − f (1)) log

R

12µ2
+

1

2
T(2)(N,−1) − 1

2
T(1)(N,−6) ,

(4.89)

where

f (2)(N) =
N∑

n=2

m(2)(n) =
5

12
N(N − 1)(N + 4)(N + 5) (4.90)

f (1)(N) =
N∑

n=2

m(1)(n) =
1

4
N(N + 1)(N + 3)(N + 4) , (4.91)

and similar definitions for the T-functions in (4.42). Since the arguments of these
functions are constant, they do not affect the equations of motion and we do not
need to give them in detailed form.

The total f -function is

fG = f (2) − f (1) =
1

6
(N4 − 8N3 −N2 − 68N)

and we observe that, like in the Maxwell case, the first two terms in the large-N
expansion of the function fG are twice the ones of a free scalar, in accordance with
the count of degrees of freedom. Thus in pure gravity, assuming Λ > 0

R = 24

√
2πΛ

G

(
1

N2
− 4

N3

)
+

(
588

√
2πΛ√
G

− 144π

G

)
1

N4
+ . . . (4.92)

Let us comment on the differences between this treatment and the one in [61],
where the linear split of the metric was used

gµν = ḡµν + hµν . (4.93)
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With this split, all the components of the metric in the York decomposition are
sensitive to the cosmological constant term. In particular, the transverse traceless
component is governed by the operator 8

−∇̄2 +
2

3
R̄− 2Λ . (4.94)

The cosmological term has the same effect as a mass and appears in the effective
action through the functions T(N,−24Λ/R). This greatly complicates the analysis,
because it introduces a new dependence of the effective action on curvature. What
is more, if Λ > 0, as one would naively expect, the cosmological term has the same
effect as a negative squared mass, with the result that the poles of the function
T(N,−24Λ/R) appear at positive rather than negative R. There are two ways of
avoiding this problem. One is to choose Λ < 0, in which case the poles occur for
negative R, as in the case of a normal massive field. Another way, that we have
followed, is to use the exponential parametrization of the metric (see also [70,71] for
a discussion on the parametrization), in which case the cosmological constant only
affects the propagation of the trace mode h, and only off shell. This effect we have
eliminated by the gauge choice h = 0. We note that if we put a gauge parameter α in
the gauge fixing term

∫
FµF

µ, the result turns out to be independent of α [69]. This
is because the sphere is “almost on shell”, in the sense that its metric satisfies nine
out of ten Einstein’s equations. Only the overall scale factor is in general off shell.
On the other hand, if we were to repeat this calculation using the linear splitting
of the metric and another gauge, the result would depend on the gauge parameters,
which is to be expected insofar as our background is not fully on shell.

Having analyzed separately all the contributions from the different quantum
fields, we will consider them together, in order to understand their interplay and
study physically realistic systems.

4.7 All together

When there is a graviton, NS scalars with mass mS, ND Dirac fields with mass mD

and NM massless gauge fields, the effective action reads

ΓN =
48πΛ

GR2
− 24π

GR
+

+
1

2
(fG(N) +NSfS(N) −NDfD(N) +NM fM(N)) log

(
R

12µ2

)
+

1

2
(NSTS(N, zS) −NDTD(N, zD)) (4.95)

where zS = 12m2
S/R, zD = 12m2

D/R and we omit constants.
We simplify the discussion by assuming that at fundamental level all fields are

massless, which could be the case if all masses are generated dynamically or by a

8Note that this operator coincides with ∆(2) on shell.
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Higgs mechanism. Then, all the T-terms in the effective action can be ignored and
the equation of motion for R is very simple

24π

GR3
(−R + 4Λ) =

1

2R
fTOT (N) (4.96)

with

fTOT = fG +NSfS −NDfD +NM fN

=
1

12
∆N4 +

2

3
∆′N3 +

1

12
∆′′N2 +

1

3
∆′′′N − 8ND , (4.97)

where

∆ = NS − 4ND + 2NM + 2

∆′ = −NS + 5ND − 2NM − 2

∆′′ = 23NS − 140ND + 34NM − 2

∆′′′ = 7NS − 50ND + 2NM − 34 (4.98)

In particular note that ∆ is the number of bosonic minus fermionic degrees of free-
dom. The solution for the Ricci scalar is given by

R± =
24π

GfTOT (N)

(
−1 ±

√
1 +

GΛfTOT (N)

3π

)

=
K±

2

N2
+
K±

3

N3
+
K±

4

N4
+O(N−5) . (4.99)

Let us now comment on the possible cases. In previous sections we have always
assumed that Λ is positive, for bosonic fields, or negative, for fermionic ones. Now
that both types of fields are present we do not make a priori any such assumption.
Then we find in general for the coefficients

K±
2 = ±48

√
π

G

Λ√
Λ

1√
∆

K±
3 = ±192

√
πΛ

G

∆′
√

∆

∆2

K±
4 = ±24

√
π

G

Λ√
Λ

48∆′2 − ∆∆′′

∆5/2
− 288π

G∆
. (4.100)

Reality of the solution requires that the product ∆Λ be positive. Thus, if bosons
dominate we must choose Λ > 0 and then in order to have positive curvature we
have to pick the solution R+. If fermions dominate we must choose Λ < 0 and the
solution R−. This is in agreement with previous assumptions. In any case, one can
achieve positive curvature, independently of the sign of the cosmological constant
in the action.
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4.8 Questions about the measure

In the paper [72], the authors also make use of a dimensionless cutoff N , but in a
more traditional field-theoretic context. In order to understand the differences, let
us first briefly describe their approach in the case of a scalar field.

The first difference is the functional measure. Whereas in our approach the func-
tional integration measure for the scalar field has been assumed to be the Fujikawa
measure [64–66]

Πxdϕ(x)(detg(x))1/4µ (4.101)

as carefully discussed in [60,61], they use the measure [73] 9

Πxdϕ(x)(detg(x))1/4(g00(x))1/2 (4.102)

with the result that the effective action (4.30) is replaced by

Γ′(g, ϕ) = SH(g) + Sm(g, ϕ) +
1

2
Tr log

(
12

R
∆

)
. (4.103)

In our approach the measure must involve an arbitrary dimensionful factor µ, that
also appears in the trace log formula, whereas in [72] the measure and the operator
appearing in the trace log are automatically dimensionless, with the result that
no external scale µ is needed. The question of determining which is the correct
functional measure in presence of gravity seems to be still an open quesion and
we refer to [75, 76] for a discussion about the physical implications of the choice of
measure, particularly in relation to diffeomorphism invariance.

Regardless of those considerations, if we compare the two formulas for the effec-
tive action we find that

Γ′(g, ϕ) = Γ(g, ϕ) − 1

2
log

(
R

12µ2
∆

)
fS(N) (4.104)

and we observe that the second term exactly removes the third term in the r.h.s.
of (4.46). Thus, for a massless scalar field, the equation of motion does not receive
any correction at one loop: the solution is R = 4Λ independently of N .

This result holds for any massless field. For a spinor ψ, a Maxwell field Aµ

(including the ghosts c and c̄) and a graviton hµν (including ghosts C̄µ and Cν) the
measures we implicitly used are the Fujikawa measures (all in four dimensions)

Πx

(
dAµ(x)(detg(x))1/8

) (
dc̄(x)(detg(x))1/4

) (
dc(x)(detg(x))1/4

)
Πx

(
dψ̄(x)(detg(x))1/4dψ(x)(detg(x))1/4

)
Πx

(
dgµν(x)dC̄µ(x)(detg(x))3/8dCν(x)(detg(x))1/8

)
(4.105)

whereas the measures advocated in [72] are 10

Πx

(
dAµ(x)dc̄(x)dc(x)g00(detg(x))1/4

)
Πx

(
dψ̄(x)dψ(x)(detg(x))3/8

)
Πx

(
dgµν(x)dC̄µ(x)dCν(x)g00(detg(x))−1

)
(4.106)

9Equivalent results would be obtained by using the measure Πxdϕ(x)(detg(x))
1/8 [74].

10Since reference [72] does not treat vector fields, for this case we use here the measure given
in [77].
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As in the case of the scalar, the effect of the additional powers of the determinant
is to make the kinetic operator appearing in the Tr log’s dimensionless and hence
to remove from the effective action the terms containing the function f , so that the
equations of motion do not get any quantum correction.

On the other hand, for massive fields (with the bare cosmological constant play-
ing the role of mass term for the gravitational field) the effective action Γ′ receives
contributions proportional to logN2m4/R2 and (N2 + logN2)m2/R, that can be
interpreted as quantum corrections of Λ/G and 1/G. (This is in sharp contrast to
our measure, with which there are no terms proportional just to 1/R or 1/R2 in the
one loop contribution.) In the presence of scalars, fermions, and the graviton, the
effective cosmological constant and Newton constant are given by

Λeff

Geff

=
ΛB

GB

− NSm
4
S

8π
logN2 +

NDm
4
D

4π
logN2 − 3Λ2

B

π
logN2 (4.107)

1

Geff

=
1

GB

−NS
m2

S

24π
(N2 + 2 logN2) +ND

m2
D

12π
(N2 − logN2) (4.108)

− ΛB

2π
(N2 + 8 logN2) .

These formulae assume that all the particles of the same type have the same mass.
If not, the main contribution to each term comes from the heaviest particles of each
type.

In the normal QFT logic, the N -dependence, which gives rise to infinitites when
N → ∞, has to be compensated by the N -dependence of the bare parameters ΛB

and GB. Then, Λeff and Geff can be interpreted as renormalized couplings, and
they must be independent of N .

If the masses of the particles are negligible with respect to the bare Planck mass,
i.e. m2

SG ≪ 1 and m2
DG ≪ 1, the dominant contribution is the gravitational one,

and it gives

Λeff ≈ 12ΛB
logN

N2
(4.109)

Geff ≈ − 2π

ΛBN2
(4.110)

One cannot choose ΛB such that Geff and Λeff are both positive.

4.9 Quantum scalar field on CP 2

There are two main assumptions in the computations above: that the space is
maximally symmetric, namely a sphere, and that all the fields are free. Of course
one could ask what would happen in different situations. Let us now look at what
happens when dropping one of the assumption. In this section we shall see what
are the implications of dealing with a spacetime which is not maximally symmetric.
Since it seems to be a sound principle to increase the difficulty one step at a time,
we focus now on a spacetime that while less symmetric than a sphere still has quite
a lot of symmetry compared to the most general solution of Einstein equations:
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CP 2. This spacetime is a solution of (Euclidean) Einstein field equations with a
cosmological constant Λ. The metric of this spacetime is [78]

gµν =
4a2

a2 + x2

(
δµν −

xµxν + x̄µx̄ν
a2 + x2

)
(4.111)

where

xµ = δµνx
ν , x̄µ = Cµνx

ν , x2 = δµνx
µxν , (4.112)

and

Cµν=


0 1 0 0
−1 0 0 0
0 0 0 1
0 0 −1 0

 (4.113)

For the classical solution the parameter a and the cosmological constant Λ are related
via

Λ =
3

2a2
(4.114)

and

R =
6

a2
(4.115)

We now follow the same recipe as in Section 4.3 and write the gravitational part of
the effective action according to (4.46) as

ΓN(R) =
36πΛ

GR2
− 16π

GR
+

1

2
fS(N) log

(
R

6µ2

)
+

1

2
TS(N, z) , (4.116)

Since for CP 2 we have [79]

λℓ =
R

6
ℓ(ℓ+ 2) + E , mℓ = (ℓ+ 1)3 (4.117)

in this case

fS(N) =
1

4
(1 +N)2(2 +N)2 (4.118)

and

TS(N, z) =
N∑
l=0

mℓ log(ℓ(ℓ+ 2) + z) (4.119)

with (assuming minimal coupling) z = 6m2

R
. The equation of motion is obtained

deriving with respect to R and reads

16π

GR3

(
−R +

9

2
Λ

)
=

1

2R

[
fS(N) − 6m2

R
SS

(
N,

6m2

R

)]
. (4.120)
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Again we can search for a solution of the form

R =
K2

N2
+
K3

N3
+
K4

N4
+ . . . (4.121)

Assuming Λ > 0 and expanding for small masses we have for the leading term

K2 = 24

√
πΛ

G
+ 12m2 +O(m4) (4.122)

Of course one could proceed in an iterative way and determine more coefficients.
What is interesting is that even though CP 2 is not a maximally symmetric space-
time, the behavior of the system is the essentially the same.

4.10 Interacting scalar field on Euclidean De Sit-

ter space

Let us now comment briefly on what happens in the case of an interacting scalar
field on the sphere, situation that has been studied in [63]11. The effective action
takes the form

ΓN(R, ϕ) = SH(R) + Sm(ϕ,R) +
1

2
TrN log

(−∇2 +m2 + 1
2
λϕ2 + ξR

µ2

)
, (4.123)

where we are assuming a λϕ4 interaction and also that the scalar is non-minimally
coupled to gravity. The quantum corrections are of the form

1

2
log

(
R

12µ2

)
f(N) +

1

2
TS

(
N,

12m2 + 6λϕ2

R
+ 12ξ

)
(4.124)

A peculiarity of this system is that the function TS can become complex. From the
effective action one can then obtain the equation of motion for the metric taking the
derivative with respect to R. Of interest is also the Hessian H, needed to study the
stability of the possible configurations. It is simply given by the second derivatives
of ΓN , thanks to the O(5) invariance of the problem. Depending on the shape of the
potential, the scalar field can have a vanishing VEV or a non-vanishing VEV. In the
first case the system is in its symmetric phase, in the second in its broken phase.
The latter is particularly complicated and we will not consider it in the following.

4.10.1 Symmetric phase

The equation of motion for the field ϕ always admits the solution ϕ = 0. In this case
the equation of motion of the metric is the same as in the case of the free massive
field that we analyzed in the beginning of this Chapter. However, this solution could
be unstable. To establish the stability of the solution it is necessary to consider the

11Also the authors of [72] have considered the case of an interacting scalar field on the sphere,
but using the functional measure (4.102). See [80].
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Hessian, evaluated at the solution. Actually what one has to consider is the density12

of the Hessian. Using everywhere the ansatz (4.48), the result is that the solution
is stable if m2 > 0. What appears to be really surprising is that the effective mass,
defined as the sum of the actual mass term and the minimal coupling term (when
going on shell the two cannot be disentangled),

m̃2
eff ≡ 1

V4

∂2ΓN

∂ϕ2

∣∣∣∣∣
ϕ=0,R=R∗

(4.125)

and the effective coupling constant

λeff ≡ 1

V4

∂4ΓN

∂ϕ4

∣∣∣∣∣
ϕ=0,R=R∗

(4.126)

are both finite and there is no need to renormalize them. Let us see how this works
more in detail. The ϕϕ component of the Hessian is

Hϕϕ = V4

[
m2 + ξR +

1

2
λϕ2 +

λR

64π2
SS +

3λ2ϕ2

16π2

∂SS

∂z

]
. (4.127)

In the symmetric phase this can be simplified to

Hϕϕ = V4

[
m2 + ξR +

λR

64π2
SS

(
N,

12m2

R
+ 12ξ

)]
. (4.128)

The density of Hessian defines the effective mass m̃2
eff . On shell R ∼ K2

N2 , that

implies z ∼ yN2 (with y = 12m2

K2
, neglecting the sub-sub-leading ξ term). Then one

obtains the finite result

m̃2
eff = m2

{
1 +

λ

32π2

[
K2

12m2
+ log

(
12m2

K2 + 12m2

)]
+O(N−1)

}
. (4.129)

Going on shell plays a crucial role in this derivation. To appreciate this fact, let us
show what would have happened proceeding in the usual quantum field theoretical
way. Now both ϕ and R have to be considered externally fixed and we are interested
in the dependence of the Hessian on the cutoff N . Taking the large N expansion of
the Hessian in the symmetric phase gives

Hϕϕ

V4
∼ m2 + ξR +

λR

64π2

[
1

6
N2 +

2

3
N − 2(6m2 + (6ξ − 1)R)

3R
logN

]
+ finite terms .

(4.130)

Defining the quantum-corrected mass and nonminimal coupling as

m2
eff ≡ 1

V4

∂2ΓN

∂ϕ2

∣∣∣∣∣
ϕ=0,R=0

(4.131)

12In the following V4 is the volume of spacetime.
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ξeff ≡ 1

V4

∂3ΓN

∂R∂ϕ2

∣∣∣∣∣
ϕ=0,R=0

(4.132)

then one has

m2
eff = m2 − λ

16π2
m2 logN +O(N0) (4.133)

ξeff = ξ +
λ

64π2

[
1

6
N2 +

2

3
N − 4

(
ξ − 1

6

)]
+O(N0) , (4.134)

so there are divergences that need to be renormalized. Inserting R ∼ K2

N2 into (4.130)
only one divergence survives, namely the logarithmic divergence that renormalizes
the mass. This result, however, is wrong. This is due to the fact that the finite
terms are not actually finite on shell! In fact, these terms are given by

finite terms =
(6m2 + (6ξ − 1)R)

3R

ψ0

5 +
√

9 − 48m2+ξR
R

2

2

+ ψ0

5 −
√

9 − 48m2+ξR
R

2

2

 ,

(4.135)

where ψ0 are polygamma functions. These polygamma functions contain some hid-
den divergences since ψ0(x) ∼ log(x) for x→ ∞ and this fact combined with setting
R = K2

N2 results in the cancellation of the logarithmically divergent term in (4.130).
In the end one obtains

m̃2
eff ≡ 1

V4

∂2ΓN

∂ϕ2

∣∣∣∣∣
ϕ=0,R=R∗

= m2 +
λ

384π2

[
K2 + 12m2 log

(
12m2

K2

)]
+O(N−1) .

(4.136)

This quantity is finite, but still different from (4.129). The reason of this mismatch
is that (4.130) contains also an infinite number of terms with inverse powers of N
that also contain R. The terms with odd powers of 1/N are of the form 1/(N2k+1Rk)
and go to zero when N → ∞, but the terms with even powers of 1/N are of the form
1/(N2kRk) and their sum gives a finite contribution. In the end the right results
is given by (4.129). A similar reasoning can be applied to the effective coupling
constant λeff . In fact, going back to the definition of λeff , we have

λeff ≡ 1

V4

∂4ΓN

∂ϕ4

∣∣∣∣
ϕ=0

= λ+
9λ2

16π2
S′
(
N,

12(m2 + ξR)

R

)
, (4.137)

The derivative of S is

S′(N, z) ≡ ∂S(N, z)

∂z
= −

N∑
ℓ=1

mℓ
1

(ℓ(ℓ+ 3) + z)2
. (4.138)

which grows logarithmically with N (remember that mℓ is cubic in ℓ). Let us now
expand S′ for large N and fixed R, as usual in QFT. Off shell the usual logarithmic
divergence is found:

λeff = λ+
3λ2

16π2
log[N ] +O(N0) . (4.139)
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This agrees with the result one would obtain using a dimensionful cutoff. Let us
now put under the microscope the supposedly O(N0) terms. They are given by

3λ2

32π2

ψ0

5 +
√

9 − 48m2+ξR
R

2

+ ψ0

5 −
√

9 − 48m2+ξR
R

2

 (4.140)

+

√
3λ2(6m2 + (6ξ − 1)R)

16π2
√

−16m2R + (3 − 16ξ)R2

ψ1

5 +
√

9 − 48m2+ξR
R

2

+ ψ1

5 −
√

9 − 48m2+ξR
R

2

 .

If the gravitational field is on shell, i.e. (4.48) holds, the arguments of the polygamma
functions become of order N and, for large N , ψ0 ∼ logN , ψ1 ∼ 1/N . Notice that
the coefficient of ψ1 is of order 1/

√
R, so those terms give finite contributions,

whereas the ψ0 terms cancel the explicit logN in (4.139). In this way we find a
finite renormalized λeff :

λeff = λ+
3λ2

32π2

[
1 + log

(
12m2

K2

)]
, (4.141)

Even though the divergences cancel, the finite part is wrong. This is because the
terms with inverse powers of N also contain inverse powers of R that, on shell, make
them finite. The correct result can be obtained most straightforwardly by using
directly the on shell expansion

S′(N, yN2) ∼ 1

6

[
1

1 + y
+ log

(
1 +

1

y

)]
+O(1/N) (4.142)

in (4.137):

λeff = λ+
3λ2

32π2

[
K2

12m2 +K2

+ log

(
12m2 +K2

K2

)]
. (4.143)

4.11 Discussion

The treatment of the cosmological constant we described in Sections 4.2–4.7 differs
from the standard one in two main ways: the most evident one is that the ultraviolet
cutoff is the dimensionless number N , rather than the usual C with dimensions of
mass. This could be just a minor difference, because one can always convert N to C,
as in (4.38). It becomes more significant when combined with the second difference,
which is the use of the semiclassical Einstein equation (4.3) before taking the limit
N → ∞. This is equivalent to using in the semiclassical Einstein equations the EM
tensor regulated with the N -cutoff, rather than a renormalized EM tensor. This im-
plies a different physical interpretation of the cutoff. One normally does not think of
the ultraviolet regulator as having physical meaning: it is merely an artificial math-
ematical device used in intermediate steps of the calculations, ultimately leading to
renormalized quantities. It is only the latter that are given physical meaning, and in
particular it is the renormalized EM tensor that is used in the semiclassical Einstein
equations (4.3). Our use of the N -regulated EM tensor looks weird, if not outright
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wrong, from this point of view. As already emphasized in [60], in the approach we
follow here the cutoff must be regarded as having a physical meaning: it is related
to the total number of degrees of freedom in the universe. The systems with finite N
are described in [60] as “gravity-coupled approximants”, systems that are physically
realizable and can give a good description of the real universe.

It is interesting to notice that a similar idea, albeit in a classical setting, was
already put forth several years ago in [81] (and also reviewed in [82] and more recently
revisited in [83]). The focus of this paper was the calculation of the self-energy of
a massive particle coupled to General Relativity. The usual way of proceeding is to
consider a point particle of mass m0 to be the limit ϵ → 0 of a shell of radius ϵ.

In such a situation the energy of the gravitational field of the particle is m0 − m2
0

2ϵ
.

Sending the cutoff to zero and solving the equation of motion generates a singular
solution with infinite self-energy. This is analogous to the standard way of computing
the cosmological constant. The idea of ADM was to use the general relativistic
equation of motion at finite ϵ [81]. The result is that the energy E of the system is
equal to the dressed mass m of the particle, E = m, and the latter is given in terms
of the bare mass and the cutoff by13

m = lim
ϵ→0

2m0

1 +
√

1 + m0

8πϵ

. (4.144)

Taking the limit ϵ → 0, the energy goes as
√
ϵ, hence an uncharged particle with

finite “bare” mass has zero physical gravitational mass and the solution it generates
is flat space. In Becker and Reuter’s calculation, the “bare” cosmological constant
is the analog of the bare mass. Also in this case the equation of motion has to be
solved for finite cutoff N and only then can the cutoff be removed, leaving flat space,
irrespective of the bare cosmological constant. The fact that the ADM calculation
is purely classical, whereas the Becker-Reuter one is quantum, does not detract
very much from the analogy: in both cases the essential point is the use of the
gravitational equation of motion before removing the regulating parameter. It is
interesting to note that a similar analogy holds in presence of interactions, too. In
the same paper, ADM also considered the case of charged particles. As they noted,
already in Newtonian physics there is the possibility that the electrostatic self-energy
of a point particle e2

4πϵ
and its gravitational self-energy −m2

2ϵ
could combine in a way

that gives a finite result. Then they actually solved Einstein equations at finite
cutoff ϵ for a point charge and obtained that the energy of the system is again given
by E = m, where now

m = lim
ϵ→0

16π

[
−ϵ+

√
ϵ2 +

( e

8π

)2
+
m0ϵ

8π

]
(4.145)

When the cutoff is sent to 0, we are left with a finite energy equal to 2|e|. Again, if
one expands the energy in e and m0 before letting ϵ→ 0, the result is the problematic
expression

m = m0 −
m2

2ϵ
+

e2

4πϵ
(4.146)

13We are setting G = 1.
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and there is no compensation since now m0 and e have to be considered as inde-
pendent parameters. Similarly, as we mentioned above, in [63] it was shown that
solving Einstein equations at finite N in the case of a self-interacting scalar fields
leads to finite quantum corrections to the mass and the coupling constant of the
scalar. It is left for the future to investigate possible generalizations to other inter-
acting theories. These results seem to suggest a relation with the idea that gravity
may be a universal regulator [84–86].

It is noteworthy that the quantum corrections do not contain any term of the
same form as the ones that are present in the classical Einstein-Hilbert action, so that
there is no renormalization of the cosmological and Newton constant. The quantum
corrections are nonlocal and can be interpreted as the terms that generate the trace
anomaly in the field equations. Another consequence is that the quantum-corrected
field equations are very different from the classical ones: actually the quantum effects
are so strong that one can have a positive curvature even if the “bare” cosmological
constant is negative. This fact could have interesting applications, that we shall not
enter into.

Another possible area of interest is the interplay between the dimensionless cut-
off N and the notion on entropy of a Lorentzian spacetime, as already remarked
by Becker and Reuter. Indeed, the sphere is the Euclidean analog of De Sitter
spacetime, which possess a classical entropy given by

S =
3π

GΛ
. (4.147)

For our purposes it is actually better to reexpress this quantity as a function of the
Hubble length ℓ as

S =
π

G
ℓ2. (4.148)

Notice that ℓ is the Lorentzian analog of the radius of a sphere. Let us consider
the case of a single minimally coupled massless free scalar field, then from (4.45)
we can obtain the square of the radius of curvature ℓ2 = 12

R
and insert this into the

expression for the entropy obtaining that

S =
π

G
ℓ2 ∼ 1

4

√
π

GΛ
N2 . (4.149)

Remembering that the total number of scalar degrees of freedom is fS(N) ∼ N4,
we can see that the entropy scales as the square root of the total number of degrees
of freedom. In their original paper, Becker and Reuter also considered another
possibility for the Energy-Momentum tensor obtaining the suggestive result

S =
1

4
fS(N) (4.150)

so in this case the entropy exactly counts (up to a numerical factor) the total number
of degrees of freedom. Moreover, it could be that the number of degrees of freedom
in the universe is actually finite, and this would result in a large although finite value
of ℓ2 and hence in a small, but non zero, value for the effective cosmological constant
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defined via Λeff = R
4

(that, in the case under examination goes like 1
fS(N)

∼ 1
N4 ).

This could maybe be put in relation with the results obtained in [87,88]. In fact, in
these papers the authors assumed that that the number of degrees of freedom in the
universe is finite and that this number is proportional to the entropy of De Sitter
spacetime, obtaining as a result that the cosmological constant has to be small. Let
us review their arguments.

The starting point is the circle amplitude ZS1 , related to the vacuum energy
density via

ZS1 =
ρVq
ℏ

, (4.151)

where Vq is the volume of spacetime. At the same time, in the worldline formalism
and after having performed a Wick rotation, we have

ZS1 =

∫ ∞

0

dτ

2τ
e−m2τZ(τ) , (4.152)

with

Z(τ) =

∫
d4qd4p

(2πℏ)4
e−

p2µτ

2 = Tr e−
p̂2µτ

2 (4.153)

Introducing two arbitrary scales λ in position space and ε in momentum space it is
possible to decompose the two integrals in a sum of integrals over finite cells with
side λ in coordinates direction and ε in the direction of momenta. The elementary
cell of phase space is then assumed to be the fundamental minimal area of phase
space, hence the identification

λε = 2πℏ . (4.154)

Spacetime and momentum space are then regulated assuming that their sizes are
given by

L = Nqλ (4.155)

M = Npε , (4.156)

with Nq and Np finite integers. Assuming one degree of freedom for each minimal
area cell in phase space, the total number of degrees of freedom is given by

N = (NqNp)
4 . (4.157)

Note also that the volume of spacetime is Vq ≃ L4. After some simple calculation,
one finds that

ρ ≲ ℏ
N

Vq
. (4.158)

Assuming that the spacetime is a De Sitter spacetime of size L, its entropy is given
by

Sgrav ∼
(
L

LP

)2

, (4.159)
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with LP the Planck length. The authors then assumed that Sgrav = N . This results
in the following bound for the vacuum energy density:

ρ ≲
ℏ

L4
PN

. (4.160)

This bound can be translated (considering the Einstein-Hilbert action on shell) in
a bound on the cosmological constant:

Λ ≲
1

L2
PN

, (4.161)

which is in agreement with the result obtained by Becker and Reuter, being N the
total number of degrees of freedom. Qualitatively this is also in agreement with the
result we obtained in this Chapter, even though we actually get that, in the case of
a single scalar field,

Λeff ∼ 1√
fS(N)

(4.162)

is inversely proportional to the square root of the total number of degrees of freedom.
An another interesting point of view is advanced in [89] (see also [90,91]), where

again the assumption (in a certain sense) that the number of degrees of freedom
in the universe is finite leads to the eventual exclusion of a positive cosmological
constant. The argument goes as follows: let us assume a quantum corpuscolar
view in which classical field configurations are limits of quantum states with large
occupation numbers. Let ℓ≫ LP be the characteristic curvature radius of a classical
gravitational field, then this field is to be considered as a coherent state of gravitons
with mean wavelength ℓ and the occupation number is

N =
ℓ2

L2
P

(4.163)

In the case of De Sitter, this can also be written as

N =
m2

P

H2
=
m4

P

Λ
(4.164)

and it is the expectation value of the number operator N̂ in the multi-particle
state |N⟩ that in the mean-field limit reproduces De Sitter spacetime. |N⟩ is a
distribution over coherent states of different frequency k, and it is assumed that the
dominant k is established by H. The idea is to show that, if at t = t0 the mean-field
description of the state |N⟩ is well reproduced by classical GR, after a certain time
the classical evolution will not be valid anymore. In practice, this means that the
expectation number of the number operator N̂ is not given anymore by (4.164).
Let us assume that the initial coherent state |N⟩ is made up only of gravitons with
frequency k = H. These gravitons can scatter, producing particles that are not in
the coherent state anymore. For example, two gravitons could interact and produce
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a new pair of particles that are not in the coherent state. Schematically, the matrix
element for this process will be given by

| ⟨N − 2, 1, 1| â†â†ââ |N⟩ |2 ∼ α2N2 ∼ 1 , (4.165)

where α ∼ H2

m2
P

∼ N−1 is the graviton-graviton coupling. Since the characteristic

momentum transfer in the process is H, the rate at which new particles outside the
coherent state are created is

Γ = Hα2N2 = H (4.166)

Given this result, we can conclude that

Ṅ ∼ −H (4.167)

After each Hubble time the state will be a little less coherent and the GR description
less trustworthy, up to a point in which the deviation becomes order one and talking
about classical De Sitter space does not make sense anymore. Since

H2 =
8π

3

Λ

m2
P

, (4.168)

as long as one has a positive Λ it is impossible to have an eternal De Sitter spacetime
and after a time

∆tmax ∼ m5
P

Λ3/2
(4.169)

the Hubble patch will evolve into a state that cannot be described anymore by
classical GR. It is worth to stress again that this results follow from the assumption
that the number N of gravitons in the coherent state is finite. An eternal classical
De Sitter is possible only if Λ → 0, limit in which N → ∞.

It is intriguing that the results quoted above, obtained in Lorentzian setting in
two completely unrelated ways, qualitatively agree with our finding of an inverse
relation between the number of degrees of freedom in the universe and the cosmo-
logical constant. This suggests that it could be of interest to repeat our computation
in the case of Lorentzian De Sitter spacetime. This is a possible line in which the
work exposed in this Thesis could be extended, another one being the investigation
of the use of the N -cutoff in presence of interacting fields.
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Chapter 5

Conclusion

The problem of reconciling gravity and quantum field theory will probably be one
of the greatest intellectual endeavors of this century.

Reframing gravity in the context of metric-affine theories allows to draw paral-
lelisms with the theories describing the other fundamental interactions and gives us
a well-founded way to construct theories that go beyond GR. This could result in
a plethora of possible phenomenological applications since in general MAG theories
contain a great number of degrees of freedom and predict the existence of several
new particles, hence several modified theories of gravity assuming the existence of
new scalars or vectors can be seen as specific examples of MAG theories. A scalar
degree of freedom contained in the distortion tensor could be the origin of the accel-
erated expansion of the universe, or the constituent of dark matter, just to name two
possibilities. Even though in this Thesis we have not directly considered the possible
phenomenological applications, our work can be seen as a first step in this direction
since we have constructed examples of healthy theories not containing ghost and
tachyons that could be good prototypes for more phenomenological works.

Another open question is the one regarding the relation between the cosmological
constant and the vacuum energy of quantum fields. The usual lore is that quantum
field theory predicts an enormous cosmological constant at odds with observations.
We have seen that using a dimensionless cutoff and computing the back-reaction of
quantum fields in a self-consistent way the result is radically different: the spacetime
tends to become flat when the cutoff is removed. Moreover, if one considers an
interacting scalar coupled to gravity and follows the same logic the effective mass
and selfcoupling of the field are both finite and do not need renormalization, at
odds with the usual results of QFT. It would be interesting to see if similar results
also hold for other interacting theories. Moreover, a possible criticism is that our
computation has been performed for a Euclidean background, while the universe
is actually Lorentzian. It is left for the future to study what happens when this
procedure is used to treat the back-reaction of quantum fields on Lorentzian De
Sitter spacetime.
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Appendix A

Standard propagators for various
fields

In this Appendix we are going to report the derivation and the final form of the
standard propagators for fields of various spin and parity, following the discussion
in [1]. Let us stress that states with same spin but different parities are different
geometric objects. The standard way of describing a spin-s object, with integer s,
is using a totally symmetric rank-s tensor. Such a state has parity (−1)s, so for
spin 0 and 2 it has even parity while for spin 1 and 3 it has odd parity. In order
to describe the other states one needs: a totally antisymmetric 3-tensor for 0−, an
antisymmetric 2-tensor for 1+, a 3-tensor that is hook-(anti)symmetric in two indices
for 2−.

A.1 Spin/parity 0+

Given the Lagrangian

L = −1

2
∂µϕ∂

µϕ− 1

2
m2ϕ2 + Jϕ , (A.1)

the Fourier transformed field equation is

(q2 +m2)ϕ = J . (A.2)

Therefore the saturated propagator is

Π =
1

2

∫
d4q

(2π)4
J(−q) 1

q2 +m2
J(q) . (A.3)

A.2 Spin/parity 0−

A degree of freedom 0− is contained in a totally antisymmetric rank three tensor.
Let us consider the following Lagrangian

L = −1

8
HµνρσH

µνρσ − 1

2
m2BµνρB

µνρ + JµνρBµνρ ,

Hµνρσ = 4∂[µBνρσ] , (A.4)
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where B is totally antisymmetric. The Fourier transform of the Lagrangian is

L = −1

2
Bµνρ

[(
q2 +m2

)
P
(
0−)+m2P33

(
1+
)]

µνρ
αβγBαβγ + JµνρBµνρ ,(A.5)

and the Fourier transformed field equation is[(
q2 +m2

)
P
(
0−)+m2P33

(
1+
)]

·B = J . (A.6)

The 1+ component vanishes on shell in absence of sources. The saturated propagator
is

Π =
1

2

∫
d4q

(2π)4
J(−q) ·

[
1

q2 +m2
P
(
0−)+

1

m2
P33

(
1+
)]

· J(q) . (A.7)

Substituting the expressions for P (0−) and P33 (1+) gives

Π =
1

2

∫
d4q

(2π)4
Jµνρ(−q) P (0−,m2)µνρ

αβγ

q2 +m2
Jαβγ(q) , (A.8)

where

P (0−,m2)µνρ
αβγ ≡ P

(
0−)

µνρ
αβγ
∣∣∣
q2→−m2

=

(
δ
[α
[µδ

β
ν δ

γ]
ρ] + 3

q[µq
[αδβν δ

γ]
ρ]

m2

)
. (A.9)

Let us now consider the massless case. The saturated propagator is then given by

Π =
1

2

∫
d4q

(2π)4
J(−q) · 1

q2
P
(
0−) · J(q) , (A.10)

and the source constraint is

P33

(
1+
)
· J = 0 . (A.11)

Using this constraint, the saturated propagator is

Π =
1

2

∫
d4q

(2π)4
Jµνρ(−q) 1

q2
ηµαηνβηργ J

αβγ(q) . (A.12)

In the massless case the projector P (1+)33 is absent,because the Lagrangian is in-
variant under the gauge transformation

Bµνρ → Bµνρ + ∂[µΩνρ] , (A.13)

where Ωνρ = −Ωρν and ∂νΩνρ = 0. This makes the 1+ components gauge degrees of
freedom.
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A.3 Spin/parity 1−

Given the Proca Lagrangian

L = −1

4
FµνF

µν − 1

2
m2AµA

µ + JµAµ , (A.14)

the Fourier transformed field equation is[
(q2 +m2)T +m2L

]
· A = J . (A.15)

Using the expressions for T and L the saturated propagator can be written as

Π =
1

2

∫
d4q

(2π)4
Jµ(−q)

P (1−,m2)µν
q2 +m2

Jν(q) , (A.16)

where

P
(
1−,m2

)
µν ≡ T µν

∣∣∣
q2→−m2

=
(
ηµν +

qµqν
m2

)
. (A.17)

Let us now consider the massless case. The saturated propagator is given by

Π =
1

2

∫
d4q

(2π)4
J(−q) · 1

q2
T · J(q) , (A.18)

and the source constraint is

q · J = 0 . (A.19)

Using this constraint for we get

Π =
1

2

∫
d4q

(2π)4
Jµ(−q) 1

q2
ηµν J

ν(q) . (A.20)

The source constraint in the massless case is related to invariance under the gauge
transformation Aµ → Aµ + ∂µϕ.

A.4 Spin/parity 1+

Since a degree of freedom 1+ is contained in an antisymmetric rank-2 tensor Bµν ,
let us consider the following Lagrangian

L = −1

6
HµνρH

µνρ − 1

2
m2BµνB

µν + JµνBµν ,

Hµνρ = 3∂[µBνρ] . (A.21)

Using the spin projectors of Chapter 2, the Fourier transform of the Lagrangian is

L = −1

2
Bµν

[(
q2 +m2

)
Pa

(
1+
)

+m2Pa

(
1−)]

µν
ρσBρσ + JµνBµν , (A.22)
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the Fourier transformed field equation is[
(q2 +m2)Pa

(
1+
)

+m2Pa

(
1−)] ·B = J . (A.23)

The 1− component vanishes on shell in absence of sources. Using the expressions
for Pa (1+) and Pa (1−) the saturated propagator can be written as

Π =
1

2

∫
d4q

(2π)4
Jµν(−q) P (1+,m2) µν

ρσ

q2 +m2
Jρσ(q) , (A.24)

where

P
(
1+,m2

)
µν

ρσ ≡ Pa(1
+)µν

ρσ
∣∣∣
q2→−m2

=

(
δ
[ρ
[µδ

σ]
ν] + 2

δ
[ρ
[µqν]q

σ]

m2

)
. (A.25)

In the massless case, Pa(1
−) drops out and the 1− components become pure gauge.

This is due to the fact that the Lagrangian is invariant under the transformation

Bρσ → Bρσ + ∂[ρξσ] . (A.26)

In this case the propagator becomes

Π =
1

2

∫
d4q

(2π)4
J(−q) · 1

q2
Pa

(
1+
)
· J(q) , (A.27)

and the source constraint is

Pa

(
1−) · J = 0 . (A.28)

The saturated propagator is

Π =
1

2

∫
d4q

(2π)4
Jµν(−q) 1

q2
ηµρηνσ J

ρσ(q) . (A.29)

A generic 2nd rank antisymmetric tensor in four dimension has 6 independent com-
ponents. Since ξ can be transverse or longitudinal, we can remove 2+3 components
and so there is only one physical degrees of freedom [92].

A.5 Spin/parity 2+

The massive Fierz-Pauli Lagrangian with a source is

L = −1

2
hµν2hµν +

1

2
h2h+ (∂µh

µν)∂νh− (∂µh
µν)∂ρhνρ +

1

2
m2(hµνh

µν − h2) + Jµνhµν .

(A.30)

Using the spin projectors of Chapter 2, the Fourier transform of the Lagrangian is

L =
1

2
(q2 +m2)hµν

[
Ps(2

+) − 2Ps(0
+, ss)

]
µν

ρσhρσ

+
1

2
m2hµν

[
Ps(1

−) −
√

3Ps(0
+, sw) −

√
3Ps(0

+, ws)
]
µν

ρσhρσ + Jµνhµν ,
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the resulting Fourier transformed field equation is[
(q2+m2)

(
Ps(2

+)−2Ps(0
+, ss)

)
+m2

(
Ps(1

−)−
√

3(Ps(0
+, sw)+Ps(0

+, ws))
)]

· h = −J .

(A.31)

Using the expressions for the spin projection operators, the saturated propagator is

Π = −1

2

∫
d4q

(2π)4
Jµν(−q) 1

q2 +m2
P (2+,m2)µν

ρσJρσ(q) , (A.32)

where

P (2+,m2)µν
ρσ ≡ Ps(2

+)µν
ρσ
∣∣∣
q2→−m2

(A.33)

= P (1−,m2)(µ
(ρP (1−,m2)ν)

σ) − 1

3
P (1−,m2)µνP (1−,m2)ρσ ,

where we used definition (A.17). Let us now consider the massless case, the saturated
propagator is given by

Π = −1

2

∫
d4q

(2π)4
J(−q) · 1

q2

(
Ps(2

+) − 1

2
Ps(0

+, ss)

)
· J(q) , (A.34)

and the sources constraints are

Ps(1
−) · J = 0 , Ps(0

+, ww) · J = 0 , Ps(0
+, sw) · J = 0 . (A.35)

These constraints are equivalent to qµJµν(q) = 0. Using this constraint for the
saturated propagator, we get

Π = −1

2

∫
d4q

(2π)4
Jµν(−q) 1

q2

(
ηµρηνσ −

1

2
ηµνηρσ

)
Jρσ(q) . (A.36)

Note that the absence of Ps(1
−) and Ps(0

+, ww) is connected to the invariance under
diffeomorphism

hµν → hµν + ∂(µξν) . (A.37)

Note also that the ratio between coefficients of Ps(2
+) and Ps(0

+, ss) is −2 : this
particular choice is the only one that ensures locality of the Lagrangian. This means
that we cannot have a local theory where only Ps(2

+) appears. To show this, one
can consider the following equation of motion (EOM)

q2
{
Ps(2

+) + c1 Ps(0
+, ss) + c2 Ps(1

−) + c3 Ps(0
+, ww)

}
· h = −J . (A.38)

Invariance under diffeomorphism implies c2 = c3 = 0. Then, expanding the remain-
ing spin projectors,

q2 hµν +
(c1 − 1)

3

(
ηµνq

2 − qµqν
)
h− qµqλh

λ
ν − qνqλh

λ
µ −

(c1 − 1)

3
ηµν qρqσh

ρσ

+
(c1 + 2)

3

qµqν
q2

qρqσh
ρσ = −Jµν . (A.39)
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To have a local EOM we need to kill the term with inverse power of q2, hence we
need c1 = −2.

The presence of Ps(0
+, ss) does not imply that in such a theory there are prop-

agating states with spin 0+.
Starting from a generic symmetric tensor we have 10 independent components, then
diffeomorphism invariance reduces them to 1 + 5, where the 1 is coming from 0+

and 5 from 2+ .
Residual gauge consists on transverse ∂(µξν)

Ps(2
+)µν

ρσ q(ρξσ) = q(µξν) −
2

3
Tµνqρξ

ρ ,

Ps(0
+, ss)µν

ρσ q(ρξσ) =
2

3
Tµνqρξ

ρ ,

and it can remove 1 + 3 components. So only 2 degrees of freedom survive and they
correspond to the two polarizations of 2+ spin states.

Changing the mass term

Let us insert a parameter b inside the mass term: 1
2
m2(hµνh

µν − b h2). Now the
Fourier transform of the Lagrangian is

L =
1

2
(q2 +m2)h · Ps(2

+) · h−
(
q2 +

(3b− 1)

2
m2

)
h · Ps(0

+, ss) · h

+
1

2
m2h ·

[
Ps(1

−) + (1 − b)Ps(0
+, ww) − b

√
3(Ps(0

+, sw) + Ps(0
+, ws))

]
· h+ J · h .

The saturated propagator is

Π = −1

2

∫
d4q

(2π)4
J(−q) ·

 1

q2 +m2
P (2+,m2) − 1

6

1

q2 +
(

7b−3b2−1
2(1−b)

)
m2

P (0+,m2)

 · J(q) ,

(A.40)

where

P (0+,m2) ≡ P (0+, ss) + 3

(
4q4 + 2(3b− 1)m2 q2 + (6b+ 1)m4

m4

)
P (0+, ww)

−
√

3

(
2q2 + (3b− 1)m2

m2

)[
P (0+, sw) + P (0+, ws)

]
.

We see that in general the theory propagates also a scalar ghost. Sending b→ 1, in
the second term its mass diverges and the ghost decouples.

A.6 Spin/parity 2−

We see from Table 2.3 that a degree of freedom 2− is contained either in a hook anti-
symmetric or a hook-symmetric 3rd rank tensor. However, such tensor contains more
than just the 2−, so we have to impose some constraints to avoid the propagation of
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the other degrees of freedom. For the massless case we impose gauge invariances to
eliminate the undesired degrees of freedom. This requirement and locality uniquely
determine the action. Then, to get the massive case we add a mass term to the
massless case and we impose the following requirement:

P (2−,m2) ≡ P11(2
−)
∣∣∣
q2→−m2

(A.41)

for the symmetric case, and the same with P (2−)22 in the antisymmetric case. By
construction, the massless case is achieved by setting to zero the mass parameter.

Using a hook-antisymmetric tensor

We deal with the massless case first. Form Table 2.3 the general Lagrangian com-
patible with hook-antisymmetry is

L = −1

2
B · q2

[
P22

(
2−)+ c1 P33

(
1−)+ c2 P22(1

+) + c3 P33(2
+) + c4 P33(0

+)

+c5 P66(1
−) + c6

(
P36(1

−) + P63(1
−)
)]

·B + J ·B .

Then we require the following invariances

Bνρσ → Bνρσ + 2∂νΩρσ − ∂ρΩσν − ∂σΩνρ =⇒ c2 = 0 , (A.42)

Bνρσ → Bνρσ + ∂σψνρ − ∂ρψνσ =⇒ c3 = c4 = 0 , (A.43)

Bνρσ → Bνρσ + ∂ν∂ρξσ − ∂ν∂σξρ =⇒ c5 = c6 = 0 , (A.44)

where Ω is antisymmetric and transverse, ψ is symmetric and transverse, ξ is trans-
verse. These transformations are constructed starting from the properties of the
field they are designed to remove. We can expand the remaining spin projectors to
obtain

L = −1

3
q2BνρσB

νρσ − 1

3
q2BνρσB

ρνσ − (c1 − 1)

2
q2Bα

α
νBβ

βν +
1

3
qµqνB

µ
ρσB

νρσ

+
2

3
qµqνB

µ
ρσB

ρνσ +
2

3
qµqνBρ

µ
σB

ρνσ +
1

3
qµqνBρ

µ
σB

σνρ +
(c1 − 1)

2
qµqνB

α
α
µBβ

β
ν

−(c1 − 1)qµqνB
µν

ρB
α
α
ρ − (c1 + 1)

2q2
qµqνqρqσB

µνλBρσ
λ + JνρσBνρσ . (A.45)

Only for c1 = −1 there is locality. Therefore, the Fouries transform of the massless
Lagrangian is

L = −1

2
B · q2

[
P22

(
2−)− P33

(
1−)] ·B + J ·B . (A.46)

Now let us consider the massive case. We add to the massless case a generic mass
term

L = −1

2
B · q2

{
P22

(
2−)− P33

(
1−)} ·B + J ·B (A.47)

−m
2

2
B ·
{
P22

(
2−)+ a1 P33

(
1−)+ a2 P22(1

+) + a3 P33(2
+) + a4 P33(0

+) + a5 P66(1
−)

+a6
(
P36(1

−) + P63(1
−)
)}

·B .
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Then, the saturated propagator is

Π =
1

2

∫
d4q

(2π)4
J(−q) · 1

q2 +m2

[
P22(2

−)+
q2 +m2

m2

(
1

a3
P33

(
2+
)
+

1

a4
P33

(
0+
)
+

1

a2
P22(1

+)

)
+

q2 +m2

a5 (q2 − a1m2) + a26m
2

(
q2 − a1m

2

m2
P66(1

−)−a5P33(1
−)+a6

(
P36(1

−)+P63(1
−)
)) ]

· J(q) .

At this point we define the term inside the square bracket as Pha(2
−,m2) and we

require

Pha(2
−,m2) ≡ P22(2

−)
∣∣∣
q2→−m2

, (A.48)

obtaining

a1 = −1 , a2 = 1 , a3 = 1 , a4 = −2 , a5 = 0 , a6 = −
√

2 . (A.49)

Therefore, the Fouries transform of the massive Lagrangian for spin 2− is

L = −1

2
B · (q2 +m2)

[
P22

(
2−)− P33

(
1−)] ·B + J ·B (A.50)

−1

2
m2B ·

[
P22

(
1+
)

+ P33

(
2+
)
− 2P33

(
0+
)
−
√

2
(
P36

(
1−)+ P63

(
1−))] ·B ,

and the saturated propagator is

Π =
1

2

∫
d4q

(2π)4
J(−q) · 1

q2 +m2
Pha(2

−,m2) · J(q) , (A.51)

where

Pha(2
−,m2) ≡ P22(2

−)
∣∣∣
q2→−m2

= P22(2
−) +

q2 +m2

m2

(
P22

(
1+
)

+ P33

(
2+
)
− 1

2
P33

(
0+
))

+
(q2 +m2)2

2m4
P66(1

−) − (q2 +m2)√
2m2

(
P36(1

−) + P63(1
−)
)
.

(A.52)

The presence of P33(1
−) does not imply that in this theory there are propagating

states with spin 1−. A generic (ha) 3rd rank tensor has 20 independent components,
and the previous invariances reduce them to 8, of which 3 come from 1− and 5 from
2− . The residual gauge invariance consists on transverse

P22(2
−)αβγ

νρσ (2qνΩρσ − qρΩσν − qσΩνρ) = 2qαΩβγ − qβΩγα − qγΩαβ ,

P22(2
−)αβγ

νρσ (qσψνρ − qρψνσ) = qγψαβ − qβψαγ ,

P22(2
−)αβγ

νρσ (qνqρξσ − qνqσξρ) = qαqβξγ − qαqγξβ − q2 Tα[βξγ] ,

P33(1
−)αβγ

νρσ (2qνΩρσ − qρΩσν − qσΩνρ) = 0 ,

P33(1
−)αβγ

νρσ (qσψνρ − qρψνσ) = 0 ,

P33(1
−)αβγ

νρσ (qνqρξσ − qνqσξρ) = q2 Tα[βξγ] ,

and it removes 1 + 1 + 1 + 3 components. So only 2 degrees of freedom survive,
corresponding to the two polarizations of 2− spin states.
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Using a hook-symmetric tensor

The procedure is the same for the case in which the 2− state is contained in a hook-
symmetric tensor. Starting with the massless case, we write a general combination
of hook-symmetric projectors:

L = −1

2
B · q2

{
P11

(
2−)+ c1 P22

(
1−)+ c2 P11(1

+) + c3 P22(2
+) + c4 P22(0

+) + c5 P55

(
1−)

+c6
(
P25

(
1−)+ P52

(
1−))} ·B + J ·B .

Then we require the following invariances

Bνρσ → Bνρσ + 2∂νψρσ − ∂ρψσν − ∂σψνρ =⇒ c3 = c4 = 0 , (A.53)

Bνρσ → Bνρσ + ∂σΩνρ + ∂ρΩνσ =⇒ c2 = 0 , (A.54)

Bνρσ → Bνρσ + ∂ν∂ρξσ + ∂ν∂σξρ =⇒ c5 = c6 = 0 , (A.55)

where Ω is antisymmetric and transverse, ψ is symmetric and transverse, ξ is trans-
verse. As before, note that these transformations are constructed starting from the
symmetry properties of the field and are designed to eliminate the undesired degrees
of freedom. Expanding the remaining spin projectors we get

L =
1 − c1

6
q2Bν

α
αB

νβ
β −

1

3
q2BνρσB

νρσ +
1

3
q2BνρσB

ρνσ − 1 − c1
3

q2Bα
ανB

νβ
β (A.56)

+
1 − c1

6
q2Bα

ανB
β
β
ν +

1

3
qµqνB

µ
ρσB

νρσ − 1 − c1
6

qµqνB
µα

αB
νβ

β −
2

3
qµqνB

µ
ρσB

ρνσ

+
1 − c1

3
qµqνB

µνρBρ
α
α − 1 − c1

3
qµqνB

ρµνBρ
α
α +

2

3
qµqνBρ

µ
σB

ρνσ − 1

3
qµqνBρ

µ
σB

σνρ

+(1 − c1)

(
1

3
qµqνB

µα
αB

β
β
ν − 1

6
qµqνB

α
α
µBβ

β
ν − 1

3
qµqνB

µνρBβ
βρ +

1

3
qµqνB

ρµνBβ
βρ

)
+(c1 + 1)

(
− 1

6q2
qµqνqρqσB

µνλBρσ
λ +

1

3q2
qµqνqρqσB

µνλBλ
ρσ − 1

6q2
qµqνqρqσB

λµνBλ
ρσ

)
+JνρσBνρσ .

Only for c1 = −1 there is locality.
Therefore, the Fourier trasform of the massless Lagrangian for spin 2− is

L = −1

2
B · q2

[
P11

(
2−)− P22

(
1−)] ·B + J ·B . (A.57)

Now we come to the massive case. We add to the massless Lagrangian a generic
mass term

L = −1

2
B · q2

[
P11

(
2−)− P22

(
1−)] ·B (A.58)

−m
2

2
B ·
{
P11

(
2−)+ a1 P22

(
1−)+ a2 P11(1

+) + a3 P22(2
+) + c4 P22(0

+) + a5 P55

(
1−)

+a6
(
P25

(
1−)+ P52

(
1−))} ·B + J ·B .

We calculate the saturated propagator and we define Phs(2
−,m2)

Π =
1

2

∫
d4q

(2π)4
J(−q) · 1

q2 +m2
Phs(2

−,m2) · J(q) . (A.59)
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Then we require

Phs(2
−,m2) = P11(2

−)
∣∣∣
q2→−m2

, (A.60)

obtaining

a1 = −1 , a2 = 1 , a3 = 1 , a4 = −2 , a5 = 0 , a6 = −
√

2 . (A.61)

Therefore, the Fourier transform of the massive Lagrangian for spin 2− is

L = −1

2
B · (q2 +m2)

[
P11

(
2−)− P22

(
1−)] ·B + J ·B (A.62)

−1

2
m2B ·

[
P11

(
1+
)

+ P22

(
2+
)
− 2P22

(
0+
)
−
√

2P25

(
1−)−√

2P52

(
1−)] ·B ,

and the saturated propagator is

Π =
1

2

∫
d4q

(2π)4
J(−q) · 1

q2 +m2
Phs(2

−,m2) · J(q) , (A.63)

where

Phs(2
−,m2) ≡ P11(2

−)
∣∣∣
q2→−m2

= P11(2
−) +

q2 +m2

m2

(
P11

(
1+
)

+ P22

(
2+
)
− 1

2
P22

(
0+
))

+
(q2 +m2)2

2m4
P55(1

−) − (q2 +m2)√
2m2

(
P25(1

−) + P52(1
−)
)
.

(A.64)

A.7 Spin/parity 3−

Singh and Hagen [93] have obtained a quadratic Lagrangian that describes a single
massive spin-3 field. It can be expressed in different ways by using different set of
auxiliary fields, but on-shell they are all equivalent. Let us consider the formulation
that requires the minimal number of auxiliary field, namely a single real scalar field,
which in four dimensional spacetime is given by

L = −1

2

[
(−Φµνρ2Φµνρ + 3Φµ2Φµ + 6 (∂ρΦ

µνρ) (∂µΦν) − 3 (∂ρΦ
µνρ) (∂σΦµνσ) − 3

2
(∂µΦµ)2

]
+ϕ(−2 + 4m2)ϕ+mΦµ∂µϕ− 1

2
m2(ΦµνρΦ

µνρ − 3ΦµΦµ) + J · Φ + j · ϕ , (A.65)

where Φµνρ = Φ(µνρ) and Φµ ≡ Φµνρη
νρ. The first line describes the massless spin 3

field.
We can first solve for ϕ through its EOM and back substitute the result into the

action. This produces the term −1
4
m2(∂µΦµ)(−2+4m2)−1(∂νΦν). Substituting this

back into the action, Fourier transforming and expressing the result in terms of the
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spin projection operators gives [94]

S = −1

2

∫
d4q

(2π)4

(
Φ ·
[
(q2 +m2)P (3−) +m2P11(2

+) − 4(q2 +m2)P11(1
−) −

√
5m2P14(1

−)

−
√

5m2P41(1
−) −

(
9

2
q2 + 2m2 − m2q2

2(q2 + 4m2)

)
P11(0

+)

−
(

1

2
q2 + 2m2 − m2q2

2(q2 + 4m2)

)
P44(0

+) − 3

(
(
q2

2
+m2) − m2q2

6(q2 + 4m2)

)
P14(0

+)

−3

(
(
q2

2
+m2) − m2q2

6(q2 + 4m2)

)
P41(0

+)
]
· Φ + J · Φ

)
. (A.66)

This gives the saturated propagator

Π =

∫
d4q

(2π)4
J ·
[ 1

q2 +m2
P (3−) +

1

m2
P11(2

+) +
4

5m4
(q2 +m2)P44(1

−)

− 1√
5m2

P (1−)14 −
1√
5m2

P41(1
−) +

1

40m6

(
(q2)2 + 7m2q2 + 16m4

)
P11(0

+)

+
1

40m6

(
9(q2)2 + 39m2q2 + 16m4

)
P22(0

+)

− 1

40m6
(q2 + 3m2)(3q2 + 8m2)

(
P14(0

+) + P41(0
+)
) ]

· J . (A.67)

Substituting the expressions for the spin projection operators gives (see, for example,
[95])

Π =

∫
d4q

(2π)4
J · P (3−,m2)

q2 +m2
· J (A.68)

where

P (3−,m2) µνρ
λτσ ≡ P (3−)µνρλτσ

∣∣∣
q2→−m2

(A.69)

= P (1−,m2)µ
λP (1−,m2)ν

τP (1−,m2)ρ
σ − 3

5
P (1−,m2)µνP (1−,m2)λτP (1−,m2)ρ

σ ,

where we used definition (A.17).
The Lagrangian for the massless spin 3 field is obtained by setting m = 0 and

ϕ = 0 in (A.65). Then, Fourier transformed action in terms of spin projection
operators is

S =
1

2

∫
d4q

(2π)4

(
q2Φ ·

[
−P (3−) + 4P11(1

−) +
9

2
P11(0

+) +
3

2
P41(0

+) +
3

2
P14(0

+)

+
1

2
P44(0

+)

]
· Φ + J · Φ

)
. (A.70)

The spin-3 gauge invariance implies the following source constraints:

P11(2
+) · J = 0 , P44(1

−) · J = 0 , P14(1
−) · J = 0 ,

[
P11(0

+) − 3P44(0
+)
]
· J = 0 .

(A.71)
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Using a gauge in which P11(0
+) ·Φ = 0 and P41(0

+) ·Φ = 0, the saturated propagator
is

Π =

∫
d4q

(2π)4
1

q2
J ·
[
− P (3−, q) +

1

4
P11(1

−, q) + 2P44(0
+, q)

]
· J . (A.72)

Substituting the expressions for the spin projectors and assuming that the source
constraints are equivalent to the condition qµJµνρ − trace = 0, one obtains

Π =

∫
d4q

(2π)4
1

q2
Jµνρ(−q)

[
− ηµληντηρσ +

3

4
ηµνηλτηρσ

]
Jλτσ(q) . (A.73)

This is in agreement with the formula (4.12) in [96]. The assumption on the source
condition follows directly from the spin-3 symmetry of the action given by δΦµνρ =
∂(µξνρ), where ξµν is traceless.
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Appendix B

Coefficients matrices

We list here the coefficient matrices appearing in the decomposition of the most
general Lagrangian for antisymmetric MAG in the Einstein form of the theory.

a(2+)33 =
1

2

(
−q2

) (
2bTT

1 + bTT
2 + bTT

4 + bTT
5

)
− 1

2

(
2mTT

1 +mTT
2

)
(B.1)

a(2+)34 =
iq3

4
√
2

(
bRT
1 + 2bRT

2 + bRT
3

)
(B.2)

a(2+)44 =
1

4

2 (
−q2

)
− 1

4
q4
(
4bRR

1 + bRR
2

)
(B.3)

a(2−)22 =
1

2
(−q2)(2bTT

1 + bTT
2 )− 1

2
(2mTT

1 +mTT
2 ) (B.4)

a(1+)22 =
1

6
(−q2)(6bTT

1 + 3bTT
2 + bTT

4 − bTT
5 + 4bTT

6 + 2bTT
7 )−mTT

1 − 1

2
mTT

2 (B.5)

a(1+)23 =
1

3
√
2
(−q2)(−2bTT

4 + 2bTT
5 + 4bTT

6 − bTT
7 ) (B.6)

a(1+)33 =
4

3
(−q2)(3bTT

1 − 3bTT
2 + bTT

4 − bTT
5 + bTT

6 − bTT
7 )− 4mTT

1 + 4mTT
2 (B.7)

a(1−)33 = (−q2)(bTT
1 +

1

2
bTT
2 + bTT

3 )−mTT
1 − 1

2
mTT

2 −mTT
3 (B.8)

a(1−)36 =
1

2
√
2
(−q2)(2bTT

3 + bTT
8 )− 1√

2
mTT

3 (B.9)

a(1−)37 = 0 (B.10)

a(1−)66 =
1

2
(−q2)(2bTT

1 + bTT
2 + bTT

3 + bTT
4 + 2bTT

6 + bTT
7 + bTT

8 )− 1

2
(2mTT

1 +mTT
2 +mTT

3 )

(B.11)

a(1−)67 = 0 (B.12)

a(1−)77 = 0 (B.13)

a(0+)33 =
1

2
(−q2)(2bTT

1 + bTT
2 + 3bTT

3 + bTT
4 + bTT

5 + 3bTT
9 )− 1

2
(2mTT

1 +mTT
2 + 3mTT

3 )

(B.14)

a(0+)35 =
iq3

4
√
2
(bRT

1 + 2bRT
2 + bRT

3 − 3bRT
4 + 6bRT

5 ) (B.15)

a(0+)36 = 0 (B.16)

a(0+)55 = −q4(bRR
1 + bRR

2 + 3bRR
3 )− 1

2

2

(−q2) (B.17)

a(0+)56 = 0 (B.18)

a(0+)66 = 0 (B.19)

a(0−) = 4(−q2)(bTT
1 − bTT

2 ) + 4(−mTT
1 +mTT

2 ) (B.20)
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Appendix C

Coefficients mapping

We give here the transformation between the Lagrangian coefficients in the Cartan
basis and in the Einstein basis.

aTT
1 =

1

4

(
m2

P + 4mTT
1

)
(C.1)

aTT
2 =

1

2

(
m2

P + 2mTT
2

)
(C.2)

aTT
3 = −m2

P +mTT
3 (C.3)

cFF
1 = 2bRR

1 + bRR
2 + 2bRR

3 − 1

4
bRT
3 − bRT

5 − 1

2
bTT
4 − bTT

6 − 1

2
bTT
8 +

1

2
bTT
9 (C.4)

cFF
3 = −bRR

1 − 3

2
bRR
2 − 4bRR

3 +
1

2
bRT
3 + 2bRT

5 + 2bTT
6 + bTT

7 + bTT
8 − bTT

9 (C.5)

cFF
4 =

1

2

(
2bRR

2 + 8bRR
3 − bRT

3 − 4bRT
5 + 2bTT

4 − 4bTT
6 − 4bTT

7 − 2bTT
8 + 2bTT

9

)
(C.6)

cFF
7 =

1

2

(
−2bRR

2 − 8bRR
3 + bRT

3 + 4bRT
5 + 8bTT

6 + 2bTT
7 + 2bTT

8 − 2bTT
9

)
(C.7)

cFF
8 =

1

2

(
4bRR

2 + 8bRR
3 − bRT

3 − 4bRT
5 − 8bTT

6 − 2bTT
7 − 2bTT

8 + 2bTT
9

)
(C.8)

cFF
16 = bRR

3 (C.9)

cFT
1 =

1

2

(
−16bRR

1 − 8bRR
2 − 16bRR

3 + 3bRT
3 + 8bRT

5 + 8bTT
6 + 2bTT

7 + 4bTT
8 − 4bTT

9

)
(C.10)

cFT
8 =

1

2

(
bRT
3 + 8bTT

6 + 2bTT
7 + 2bTT

8

)
(C.11)

cFT
9 = 2bRR

2 + 8bRR
3 − 1

2
bRT
3 − 2bRT

5 − 4bTT
6 − bTT

7 − bTT
8 (C.12)

cFT
13 =

1

2

(
4bRR

2 + 16bRR
3 − bRT

3 − 8bRT
5 − 8bTT

6 − 2bTT
7 − 4bTT

8 + 4bTT
9

)
(C.13)

cTT
1 =

1

4

(
4bRR

1 + bRR
2 − bRT

3 + 4bTT
1 + 2bTT

4

)
(C.14)

cTT
2 =

1

2

(
−4bRR

1 − 3bRR
2 − 8bRR

3 + bRT
3 + 4bRT

5 + 2bTT
2 + 4bTT

6 + 2bTT
7 + 2bTT

8 − 2bTT
9

)
(C.15)

cTT
3 = bRR

2 + 4bRR
3 − 2bRT

5 + bTT
3 + bTT

9 (C.16)

cTT
5 = 4bRR

1 + 2bRR
2 + 4bRR

3 − bRT
3 − 2bRT

5 + bTT
5 − 2bTT

6 − bTT
7 − bTT

8 + bTT
9 (C.17)
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